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Abstract. In this article, we study the time-reversal properties of a generic
Markovian stochastic field dynamics with Gaussian noise. We introduce a con-
venient functional geometric formalism that allows us to straightforwardly gen-
eralize known results from finite dimensional systems to the case of continuous
fields. We give, at field level, full reversibility conditions for three notions of
time-reversal defined in the first article of this two-part series, namely T-, MT-,
and EMT-reversibility. When the noise correlator is invertible, these reversibil-
ity conditions do not make reference to any generically unknown function like
the stationary probability, and can thus be verified systematically. Focusing on
the simplest of these notions, where only the time variable is flipped upon time
reversal, we show that time-reversal symmetry breaking is quantified by a single
geometric object: the vorticity two-form, which is a two-form over the func-
tional space F to which the field belongs. Reversibility then amounts to the
cancellation of this vorticity two-form. This condition applies at distributional
level and can thus be difficult to use in practice. For fields that are defined on
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a spatial domain of dimension d =1, we overcome this problem by building a
basis of the space of two-forms Ω2(F). Reversibility is then equivalent to the
vanishing of the vorticity’s coordinates in this basis, a criterion that is readily
applicable to concrete examples. Furthermore, we show that this basis provides
a natural direct-sum decomposition of Ω2(F), each subspace of which is asso-
ciated with a distinctive kind of phenomenology. This decomposition enables
a classification of celebrated out-of-equilibrium phenomena, ranging from non-
reciprocal (chaser/chased) interactions to the flocking of active agents, dynamical
reaction-diffusion patterns, and interface-growth dynamics. We then partially
extend these results to dimensions d > 1. Furthermore, we study several notions
of entropy production and show, in particular, the entropy production rate to
be a linear functional of the vorticity two-form, which implies that the factors in
our decomposition of Ω2(F) can be interpreted as independent sources of entropy
production. Finally, we discuss how extending our results to more general situ-
ations could provide a natural framework for the generic study of the notoriously
diverse and surprising behavior of active systems at their boundaries. The geo-
metric framework offered in this paper is illustrated throughout by reference to
particular models that break time-reversal symmetry, such as Active Model B.

Keywords: dynamical processes, exact results, fluctuating hydrodynamics,
stochastic thermodynamics
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1. Introduction

Spatially extended physical systems are often best described by field theory, an approach
that has led to a wide range of applications, from the description of the superconducting
phase transition to weather forecasting and the design of large-scale civil-engineering
infrastructure. When field theory serves as a large-scale, long-time representation of
underlying degrees of freedom, fluctuations naturally arise alongside the deterministic
trend and taking them into account is the purpose of statistical field theory. Such an
emergent field theory can be derived either through explicit coarse-graining—often a
tedious and inexact process—or phenomenologically postulated based on the system’s
symmetries. Notably, when a system’s statistics exhibit time-reversal symmetry (TRS) –
such as when it is at or near thermodynamic equilibrium—the construction and analysis
of the field theory are greatly simplified in both approaches. While early applications of
statistical field theory generally obeyed this symmetry, recent decades have witnessed
growing interest in irreversible systems, often driven by biological motivations [1–3].
Bridging the theoretical gap between equilibrium and out-of-equilibrium systems has
sparked a vast body of literature focused on understanding the breakdown of TRS
itself [4–14], although most of the attention has been dedicated so far to the simpler
case of finite-dimensional systems.

In this context, two key questions arise: (1) How to determine whether a given
field theory is reversible? (2) How does TRS breakdown manifest phenomenologically?
These questions represent critical milestones that remain incompletely understood. This
article is the second in a two-part series. The first part [15] was devoted to systematically
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exploring various types of TRSs in stochastic systems with a finite number of degrees of
freedom. This second part extends and adapts these results to field theory, with a focus
on addressing the aforementioned questions (1) and (2), and in doing so, it notably
provides the foundation for a classification of out-of-equilibrium field theories.

Question (1) is notoriously related to determining whether a (possibly vector-valued)
map ζ = (ζi(r, [ϕ]))i—that is both a function of a spatial variable r and a functional
of the considered field ϕ—is the functional derivative of a free energy F [ϕ], i.e. if
ζ = δF/δϕ. However, the first issue is that, unlike in systems with finitely-many degrees
of freedom, we are not aware of any systematic approach in the literature that allows
identifying, in a generic stochastic PDE, the functional ζ that needs to derive from
a free-energy for the dynamics to be time-reversible. We fill this gap here by intro-
ducing convenient notations that allow to straightforwardly extend the knowledge
from finite dimension [15]. Furthermore, the popular approach to tackle the afore-
mentioned integrability issue has consisted—until quite recently—in guessing a fairly
general form of the free energy F [ϕ], then taking its functional derivative, and finally
deducing the corresponding constraints over ζ. While this approach works well when ζ
and F are sufficiently simple [16, 17], it can quickly become impractical. In recent
years, it was understood that a more systematic criterion to answer this question
was given by a functional version of the Schwarz condition [12, 13, 18]: ζ is integ-
rable iff δζi(r, [ϕ])/δϕ

j(r ′) = δζj(r
′, [ϕ])/δϕi(r) in a distributional sense, i.e. iff, for all

δϕ1(r),δϕ2(r),∑
i,j

ˆ [
δζi (r, [ϕ])

δϕj (r ′)
− δζj (r

′, [ϕ])

δϕi (r)

]
δϕj1 (r

′)δϕi2 (r)drdr
′ = 0 . (1)

Despite its systematic nature, since this criterion is distributional, it can be highly non-
trivial to deduce the constraints that follow from (1) on e.g. the coefficients of ζ in cases
when the latter is a gradient expansion in ϕ. To solve this problem, we here reformulate
condition (1) in a more geometric form, generalizing the approach developed for two
specific examples in a previous paper by one of us [14]. The resulting integrability
condition consists in the cancellation of a functional two-form, the vorticity two-form,
which is a vector (with additional properties) that lives in a certain functional space
Ω2(F). Exhibiting a basis of the corresponding space then makes the distributional
condition (1) equivalent to the cancellation of the components of this vector on that
basis, a more algebraic formulation of the integrability condition that turns out to
be readily applicable. In this article, we exhibit such a basis for the case of a local
functional3 ζ in one spatial dimension, and partially generalize our result to higher
dimensions.

Besides, if the existence of a free energy in reversible systems grants access to gen-
eric methods for analyzing their phenomenology, that of out-of-equilibrium systems are
generally examined case by case, hence addressing only anecdotally the generic aspect
of question (2). Remarkably, the approach we adopt to solve problem (1) provides a par-
tial yet interesting answer to question (2) as well, since we show that a phenomenology

3 See below equation (20) for the definition of local functionals.
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can be attributed to each element of the aforementioned basis. Further, in one spatial
dimension, this basis can be split into three subfamilies, each generating a subspace of
Ω2(F) that we respectively call the antisymmetric, self-symmetric, and inter-symmetric
subspace, and denote by A, Sself , and Sinter. The combination of these three subspace
hence provides a direct-sum decomposition of the space of two-forms:

Ω2 (F) =A⊕Sself ⊕Sinter . (2)

The phenomenology within each of these three subspaces turns out to be quite robust
and generic: the antisymmetric subspace typically corresponds to systems with non-
reciprocal interactions, while the inter-symmetric one is related to flocking, and the
self-symmetric subspace gathers field dynamics like that of Active Model B (AMB) or
the Kardar-Parisi-Zang (KPZ) equation, which display anisotropic propagation of fluc-
tuations. The decomposition (2) – and its extension (135) to more general situations—
thus paves the way for a classification of out-of-equilibrium stochastic field theories.

Among the set of observables quantifying irreversibility at field level, entropy pro-
duction plays a special role [14, 17]. The question of its relation with the vorticity
two-form hence arises naturally. In this article we prove that, as in finite dimension [9,
15], the loop-wise entropy production4 and the entropy production rate are both lin-
ear functional of the vorticity two-form, hence emphasizing the central role played by
the latter in the analysis of TRS breakdown. Interestingly, this also implies that the
elements of the decomposition (2) – and its generalization (135) – can be interpreted
as independent sources of entropy production. These results hold for the usual notion
of entropy production—that we here call the bare entropy production—that compares
the statistics of field trajectories to their time-reversal. Nevertheless, we show that in
certain situations, like when the field follows a conservation equation, there exists an
extended notion of entropy production, which directly takes into account the statistics
of the current associated to ϕ, and that is greater or equal to the bare one, the difference
between the two being invisible from observations solely of the field statistics and hence
from the vorticity two-form.

Time reversal, for a given stochastic dynamics, is a context dependent notion [15].
In the simplest cases it solely amounts to reversing the time variable. In other dynamics
it also requires us to flip some degrees of freedom, as is the case for e.g. momentum
variables in underdamped models. Finally, it can also require us to directly reverse a
part of the ‘force field’ that is applied to the system, like a magnetic field for instance.
In the first article [15] of this two-part series, we respectively called these three types
of time reversal T-, MT-, and EMT-reversals, the letters T, M, and E standing for
‘time’, ‘mirror’, and ‘extended’ (see [15] for details). Just as in the finite dimensional
setting, MT- and EMT- reversibility do not reduce to a single integrability condition,
as opposed to the case of T-reversibility. In this article, we give for the first time general
reversibility conditions for a stochastic field dynamics to be EMT-reversible (this notion
of time reversal subsuming the two others).

4 This is the entropy produced along a loop in function space, i.e. during one period of a cyclic evolution of the field configuration.
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The article is structured as follows. We start by describing in section 2 the type of
field dynamics we will focus on, together with the notations that will be used to extend
known finite-dimensional results—in particular those of our companion paper [15]. We
then progressively introduce in section 3 the theoretical machinery—in particular a
functional exterior calculus—that we will use later to study TRS breakdown in the
considered field theories. Throughout the development of our theoretical framework,
we illustrate its various components on a fixed example: a nonequilibrium model of
phase separation. In section 4, which is the culmination of this article, we uncover a
basis of vorticity two-forms in one spatial dimension. As announced above, the latter
first allows us to turn the previously distributional reversibility condition into a readily-
applicable, algebraic one. We then show that the resulting basis can be divided into
three subfamilies, each one having a particular kind of phenomenology. This allows a
classification of out-of-equilibrium field theories in one spatial dimension, going from
non-reciprocally interacting systems, to irreversible reaction-diffusion systems, flocking,
and interface growth. We then partially extend these results for spatial dimensions
higher than one. We also discuss how generalizing the decomposition of the space Ω2(F)
could account for some of the notoriously surprising behaviors of active systems at their
boundaries. In section 5, we connect our work to various notions of entropy production
considered in the previous literature [6, 7, 9, 19] and some new ones. Finally, while the
main focus of sections 3–5 is on T-reversal, we give in section 6 reversibility conditions
for the more general notions of MT- and EMT-reversibility and for dynamics in which
the space to which the field belongs is not simply-connected.

2. General context and notations

This section describes the class of stochastic partial differential equations (SPDEs)
whose irreversibility we shall study in the following. These SPDEs will consist of fairly
general PDEs perturbed by a Gaussian random field with zero mean, delta-correlated
in time, and arbitrarily correlated in space.

SPDEs are notoriously difficult to define in general [20–22], and we will not attempt
to provide a comprehensive definition here. However, we will construct our framework
so as to avoid the pitfalls already encountered in finite dimensions—as identified in part
I [15]—in the geometric study of the irreversibility of stochastic differential equations
(SDEs).

We begin in section 2.1 by briefly summarizing the main issues that arise in the
physical description of SDEs. In section 2.2, we introduce notations that will facilitate
extending the finite-dimensional approach developed in part I to the infinite-dimensional
setting of field theory, by analogy.

2.1. Physical description of SDEs

In this section, we recapitulate how to describe a SDE in a way that is physical, cov-
ariant, and independent of the stochastic prescription (see part I [15] for more details).

https://doi.org/10.1088/1742-5468/add0a2 7

https://doi.org/10.1088/1742-5468/add0a2


Geometric theory of (extended) time-reversal symmetries in stochastic processes: II. Field theory

J.S
tat.

M
ech.(2025)

053204

Let us consider a stochastic process xt on a finite-dimensional manifoldM, satisfying
the following SDE for a given stochastic integral prescription ε0 ∈ [0,1] (e.g. ε0=0 and
1/2 correspond to the Ito and Stratonovich conventions, respectively):

ẋt =A(ε0)+bαη
α
t . (3)

This dynamics may, for instance, describe the evolution of the positions of N particles in
R3—in which case xt = (r1(t), . . . ,rN (t)) and M= R3N—interacting with each other and
in contact with a thermal bath. In equation (3), the ηαt are real Gaussian white noises

with zero mean and correlations 〈ηαt η
β
t′〉= 2δαβδ(t− t ′); the bα(xt) are vector fields on

M, and A(ε0)(xt)—which is not generally a vector field5—is the so-called ‘ε0-drift’.
The dynamics (3) can equivalently be rewritten in any stochastic prescription ε, in

which case the new drift takes the form Ai
(ε) =Ai

(ε0)
+2(ε0− ε)bjα∂jb

i
α. The true physical

drift of the process—which can be interpreted as a force field (up to mobility) – should
not depend on the chosen prescription. Building on the case of a Langevin equation at
uniform temperature but with inhomogeneous mobility, earlier works [23, 24] identified
a suitable candidate (in an orthonormal frame) as A≡A(ε)− s(ε), where

si(ε) ≡ ∂jb
j
αb

i
α− 2εbjα∂jb

i
α , (4)

is the so-called ‘ε-spurious drift’.
Although constructed to be independent of ε, one can show that A is not a con-

travariant vector field, and therefore cannot be interpreted as a physical force field. In
part I [15], we showed that in order to correct this lack of covariance, one must choose
a (positive) reference measure on M, denoted λ= λ(x)dx1 . . .dxn, and define a ‘λ-drift’
aλ ≡A−hλ, where

hiλ ≡ biαb
j
α∂jλ , (5)

is called the ‘λ-gauge drift’. This allows one to rewrite the SDE (3) in the following
form:

ẋt = aλ+ s(ε)+hλ+bαη
α
t , (6)

where aλ is now indeed a (contravariant) vector field on M, independent of the
stochastic prescription ε, and can thus be interpreted as a force field.

This is done at the cost of choosing a reference measure λ. The latter plays the role
of a prior or a gauge, depending on whether one aims to construct an SDE from a given
‘force field’ a and noise bαη

α, or to analyze a given SDE. In the former case, our work
suggests that in addition to specifying the drift a and the noise bαη

α, it is necessary to
choose a ‘prior’ measure λ corresponding to the physicist’s a priori assumption about
the system’s state of maximal disorder (or minimal information), and then impose
aλ ≡ a. In particular, in the absence of a ‘force field’, i.e. when a= 0, the stationary

5 The transformation law of A(ε0) under coordinate changes is determined by the chain rule associated with the prescription ε0. It
is therefore a genuine vector field only when ε0 = 1/2 (Stratonovich).
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distribution is then given by λ/
´
Mdλ. In the latter case, λ is simply a gauge choice

that affects the λ-drift aλ but not physical observables such as entropy production.
Throughout the remainder of this article, we fix the reference measure λ once and

for all, and will therefore omit the λ subscript on aλ for clarity.

2.2. Extension to SPDEs

In order to generalize the finite dimensional results of [15], we first need to identify
the field-theoretic counterpart of each finite-dimensional geometric object involved in
studying the time-irreversibility of (6).

2.2.1. General setting. Let us consider a time-dependent field ϕt : Rd1 → Rd2 that
evolves on a time interval t ∈ T≡ [0,T ] according to a SPDE (7), which is Stratonovich-
discretized in space6, and ε ∈ [0,1]-discretized in time. Having the finite-dimensional
formulation (6) in mind, we write this SPDE as

∂tϕ(r, t) = a(r, [ϕ])+hλ (r, [ϕ])+ s(ε) (r, [ϕ])+

d3∑
i=1

ˆ
dr ′bi (r,r

′, [ϕ])ηi (r ′, t) , (7)

where η(r, t)≡ (η1(r, t), . . .ηd3(r, t))> is a random Gaussian field on Rd1, taking values
in Rd3, of zero mean and correlations given by 〈ηi(r, t)ηj(r ′, t ′)〉= 2δijδ(r− r ′)δ(t− t ′),
and b(r,r ′, [ϕ])≡ (b1(r,r

′, [ϕ]), . . . ,bd3(r,r
′, [ϕ])) is a kernel operator sending Rd3-valued

fields to Rd2-valued fields over Rd1. In order to study dynamics (7) in both a covariant7

and discretization-free way, just as in the finite-dimensional situation (6), we have split
the deterministic drift of equation (7) into three terms: a time-discretization-dependent
spurious drift s(ε)(r, [ϕ]), a λ-gauge drift hλ(r, [ϕ]), and a λ-drift a(r, [ϕ]) (the latter
two being independent of ε), where λ is a reference-measure over the functional space—
denoted by F—to which ϕ belongs. We will denote by bϕ, b[ϕ], or simply b when
there is no ambiguity, the operator associated to the kernel b(r,r ′, [ϕ]), i.e. bϕη(r)≡´
b(r,r ′, [ϕ]) ·η(r ′)dr ′ =

∑
i

´
bi(r,r

′, [ϕ])ηi(r ′)dr ′, where dr≡ dr1 . . .drd1 denotes the
Lebesgue measure on Rd1.

To generalize more easily the finite-dimensional results from [15] to this field-
theoretic context, we are going to formally ‘geometrize’ the dynamics (7). This first
means that we regard the functional space F as an infinite dimensional manifold on
which the dynamics takes place. We further denote by TϕF its tangent space at any
ϕ, which can be thought of as the space of small fluctuations around ϕ, and whose
structure will be further detailed shortly. In turn, a is a vector field over F, i.e. for all
ϕ ∈ F, a[ϕ]≡ a(·, [ϕ]) is a tangent vector belonging to TϕF. In this perspective, the spa-
tial variable r plays the role of a continuous coordinate index so that, for instance, the
vector a[ϕ] ∈ TϕF has coordinates airϕ = air[ϕ]≡ ai(r, [ϕ]), where i ∈ [[1,d2]] and r ∈ Rd1.

6 Stating that each spatial differential operator is defined as a limit of a midpoint-discretized operator is actually not sufficient to
fully characterize the limit SPDE [24], but we will disregard such questions in this article. In particular, we will assume that the
usual chain rule applies to spatial derivatives, hence the term ‘Stratonovich-discretized in space’.
7 Here the covariance is with respect to a change of chart over the function space F to which ϕ belongs. For instance, going from
Cartesian to spherical coordinates in Rd1 amounts to a change of chart on F, since it gives a different coordinate expression of a
field ϕ(r1, . . . ,rd1 )→ ϕ̃(r,θ1, . . . ,θd1−1).
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Furthermore, we will use the following generalized Einstein convention: in addition to
summing over repeated discrete indices, we will also implicitly integrate over repeated
continuous variables, when written as indices. Dynamics (7) then reads

∂tϕ
ir = air [ϕ] +hirλ [ϕ] + sir(ε) [ϕ] + birjr ′ [ϕ]ηjr

′
, (8)

or, if we stack together the discrete indices:

∂tϕ
r = ar [ϕ] +hr

λ [ϕ] + sr(ε) [ϕ] +br
r ′ [ϕ] ·ηr ′

. (9)

These conventions allow us to deduce the coordinate expression of the spurious and λ-
gauge drift directly from their finite dimensional counterparts (4) and (5): they respect-
ively read

si1r1(ε) ≡ δ

δϕi2r2
bi2r2i3r3

bi1r1i3r3
− 2εbi2r2i3r3

δ

δϕi2r2
bi1r1i3r3

, (10)

and

hi1r1 = bi1r1i3r3
bi2r2i3r3

δ

δϕi2r2
λ . (11)

The only kind of (functional) coordinate charts on the manifold F that we consider here
correspond to choosing an arbitrary coordinate system on Rd1 and any basis in Rd2. In
particular, this implies that if we choose the Lebesgue measure on F as the reference
measure λ, then whatever the functional coordinate chart, λ is independent of ϕ and
hence the λ-gauge drift hλ vanishes8.

Similarly, if the operator b does not depend on ϕ, the spurious drift s(ε) is identically
zero. When this is not the case, some diverging terms may appear that should then be
taken care of by a proper spatial-discretization scheme [24]. For instance if ϕ is a scalar
field, i.e. d2=1, and

brjr ′ =
√
M (ϕ(r ′))∂r′jδ (r− r ′) , (12)

with M a mobility, then

br
r ′ [ϕ] ·ηr ′

= brjr ′ [ϕ]ηjr
′
=

ˆ
dr ′
[√

M (ϕ(r ′))∂r′jδ (r− r ′)
]
ηj (r ′)

=−∇ ·
√
M (ϕ(r))η (r) , (13)

while the spurious drift formally reads (see appendix A)

8 What we say about the ‘functional Lebesgue measure’ λ≡Dϕ should be understood in a discretized setting. For instance,
discretizing (ϕi(r))i=1...d2 at given sites rα ∈ Rd1 gives (ϕiα)i,α, and the ‘functional Lebesgue measure’ approximately reads λ' λ̃≡∏

i,α dϕ
iα in the canonical basis of Rd2 . If we now change basis in Rd2 , a prefactor appears in the expression of λ̃. But the latter is

independent of ϕ, hence the discrete version of the λ-gauge drift vanishes whatever the spatial discretization and we can consider
its continuous limit hλ to be equally vanishing.
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sr1(ε) = (1− ε)
∑
i

ˆ
dr2

[
∂ri2δ (r1− r2)

] [
∂ri3
δM (ϕ(r2))

δϕr3

]∣∣∣∣
r3=r2

. (14)

The issue is that the last term in squared brackets in equation (14) is ill defined. But if
we go back to its discretized version, assuming d1=1 to simplify notation, it takes the
form: [

∂ri3
δM (ϕ(r2))

δϕr3

]∣∣∣∣
r3=r2

=M ′ (ϕ(r2))

[
∂ri3
δϕr2

δϕr3

]∣∣∣∣
r3=r2

→M ′ (ϕ(k2))
1

2

[
∂ϕ(k2)

∂ϕ(k2+1)
− ∂ϕ(k2)

∂ϕ(k2− 1)

]
, (15)

hence it clearly vanishes.
Using the conventions introduced above, the Fokker-Planck equation associated

to (8) reads

∂tPt [ϕ] =− δ

δϕir
J irt , (16)

where Pt[ϕ] is the probability density (with respect to the Lebesgue measure on F) of
the solution to equation (8) at time t, and Jt is the corresponding functional probability
current, which is a vector field over F and whose coordinate expression is

J irt ≡ air [ϕ]Pt−Dir,jr ′ δ

δϕjr ′Pt . (17)

In the expression (17) of the probability current, D is the diffusion operator, defined by

Dir,jr ′ ≡ birkr ′ ′b
jr ′

kr ′ ′ , (18)

or, in operator notations, D= bb†, were b† stands for the L2-adjoint of b for the
Lebesgue measure on Rd1 and the canonical scalar products of Rd2 and Rd3. Throughout
this article, we assume that the stationary probability measure Pss[ϕ] exists and is
unique.

A pivotal object in our study of the time-reversal properties of dynamics (8) will
be D−1a. Note that our results can be (at least partially) extended when D is not
invertible, as we did in the finite dimensional setting in [15]. But for simplicity, up
to section 6, we will assume below that D−1a is always well defined. In particular,
this requires that aϕ belongs to the image of bϕ, Im(bϕ). Consequently all the drifts
applied to ϕ in equation (8) are included9 in Im(bϕ) and hence the smallest functional

9 Note that the whole right-hand side of a stochastic dynamics (6) is generically a tangent vector field only in the Stratonovitch
prescription, for which we see that s(1/2) +hλ indeed belongs to Im(bx). We here extrapolate this phenomenon, known for SDEs [25,
26], to SPDEs.
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manifold F in which the solutions of equation (8) are confined is imposed by Im(bϕ), i.e.
TϕF= Im(bϕ). Regarding the global topology of F, we likewise assume, up to section 6, it
is simply-connected. We stress that, although the field ϕ is defined on Rd1 for simplicity,
our approach can be adapted to any boundary-less smooth manifold without major
difficulty.

2.2.2. A running example: the active model B. For the sake of concreteness, as we
develop our somewhat abstract theoretical framework in sections 3–5, we will repeatedly
illustrate most of its various components on a fixed example, the so-called AMB, which
is arguably the simplest field theory to show out-of-equilibrium phase separation [16,
17]. The AMB dynamics takes the form:

∂tρ(r) =∇·
[
M∇µ(r, [ρ])+

√
Mη

]
. (19)

In equation (19), M is a constant scalar mobility, η(r, t) a Gaussian random field
identical to that of equation (8), and µ(r, [ρ]) is a chemical potential defined, in the
spirit of Landau-Ginzburg theory, as a second order expansion in the gradient of ρ:

µ(r, [ρ])≡ αρ(r)+βρ(r)3+λ(ρ(r)) |∇ρ(r) |2−κ(ρ(r))∆ρ(r) , (20)

where α and β are constants, while, generalizing slightly [16], we choose λ and κ
to be strictly local functionals of ρ. In this article, a map µ(r, [ρ]), which is both a
function of a spatial variable r and a functional of a field ρ, will be said to be local
if it depends on the value of ρ and of its derivatives up to a finite order q at r,

µ(r, [ρ]) = µ
(
ρ(r), ∂ρ(r)∂ri , . . . ,

∂qρ(r)

∂ri1 ...∂riq

)
, and strictly local if it is local with q =0. With

the notations used to describe dynamics (8) above, of which the AMB dynamics is
a particular instance, the reference measure is taken to be the Lebesgue measure so
that hλ = 0. The λ-drift reads ar[ρ] =∇·M∇µ(r, [ρ]), while the operator b takes the

form br
′

ir =−
√
M ∂

∂ri δ(r− r ′), which in particular implies that the spurious drift van-
ishes for any time-discretization scheme, s(ε) = 0, and that the diffusion operator reads

Drr ′
=−M∆δ(r− r ′). Note that, in this case, as assumed for the more general dynam-

ics (8), D−1a=−∆−1∆µ is well defined and coincides with minus the chemical potential
µ. Finally, we stress that this example also satisfies the general hypothesis on the simply-
connectedness of F. Indeed, the constraint over the space F in this case is essentially
the conservation of a given total ‘mass’ m=

´
Rd1
ρ. Hence, if we take ρ1,ρ2 ∈ F, any

convex linear superposition shares the same global mass m, and thus also belongs to F.
It follows that F is convex, and consequently simply-connected.

3. Quantifying time-irreversibility through the vorticity two-form

In this section, we study the presence or absence of TRS in the dynamics (7) or equival-
ently (8). In [14], one of us introduced for this purpose a functional exterior derivative
for scalar field, which generalizes the finite-dimensional exterior derivative—the latter
being itself a generalization of the curl operator of vector analysis to dimensions higher
than three. In section 3.1, we start by extending this construction to the more general

https://doi.org/10.1088/1742-5468/add0a2 12

https://doi.org/10.1088/1742-5468/add0a2


Geometric theory of (extended) time-reversal symmetries in stochastic processes: II. Field theory

J.S
tat.

M
ech.(2025)

053204

context of the vector-valued field ϕ obeying equation (8). This then allows us to define a
functional vorticity two-form (alternatively called a functional cycle-affinity two-form),
denoted by ω, that generalizes to field theory the corresponding objects already intro-
duced for Markov chains [10, 27] and finite dimensional stochastic processes [9]. In
section 3.2, we introduce two differential operators, the cycle-affinity operator ω̂ and
the vorticity operator W, that are both dual to the vorticity two-form ω. While the
benefits of introducing the former operator will only appear in section 4.3, we show
below that the latter can be used to gain insight into the out-of-equilibrium phenomen-
ology of the dynamics (8) under study.

3.1. Reversibility condition and functional exterior derivative

Up until section 6, we assume that all the components of the field ϕ are even under
time-reversal. Dynamics (8) is then said to be time-reversal symmetric when, in steady
state, it has the same probability to travel any trajectory (ϕt)t∈T forward and back-
ward in time10. This reads P[(ϕt)t∈T] = P[(ϕT −t)t∈T], where P is the (stationary) path
probability associated to dynamics (8). Just as in finite dimension [6, 9, 28–30], this
time-reversibility property is equivalent to the cancellation of the stationary probability
current Jss = aPss−DδPss/δϕ, a property that can be straightforwardly reformulated
as

D−1a=
δ lnPss

δϕ
. (21)

In other words, time-reversibility of dynamics (8) amounts to a (functional) integrability
constraint11 over D−1a. The reversibility condition (21) has been argued [13] to be
equivalent to D−1a satisfying the functional integrability condition:

δ
[
D−1aϕ

]
ir

δϕjr ′ −
δ
[
D−1aϕ

]
jr ′

δϕir
= 0 , (22)

in a distributional sense, for all ϕ ∈ F, with [D−1aϕ]ir standing for [D−1a]ir[ϕ] =

[D−1
ϕ ]irjr ′ajr

′

ϕ . While the authors of [13] proved that equation (21) implies equation (22),
the simply-connectedness of F was assumed to be enough for the reciprocal implication
to be valid, as in finite dimension. Among other things, the formalism introduced below
allows us to prove this is indeed the case.

We here emphasize that our analysis of functional integrability is conducted with
significantly greater mathematical rigor than our treatment of stochastic PDEs in this

10 We also assume that the time-reversal of dynamics (8) does not involve any direct modification of the drift and diffusion operator,
as it would happen e.g. in the presence of an external magnetic field. In the language used in paper I [15], this means that we
only focus on T-reversal until section 6 where we consider EMT-reversal. Besides, at least when the field ϕ is conserved, one can
also define a resolved notion of reversibility where, together with the statistics of the field, those of the corresponding current are
explicitly considered (see section 5.2).
11 There is also an normalizability constraint over the potential from which D−1a derives. But in practice, just as in finite dimen-
sion [15], we only need the kernel of the Fokker-Planck operator, P 7→ − δ

δϕir
[airP −Dirjr ′ δ

δϕjr
′ P ], to be one-dimensional, not that

any of these stationary measures integrates to one. Thus, without loss of generality, we will disregard this normalizability constraint
throughout this article.
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article. This level of rigor—necessary to draw strong physical conclusions later on—
justifies the formal nature of some of the sections that follow.

3.1.1. Functional one-forms. In order to fully prove and interpret the equivalence
between equations (21) and (22), and also to exploit the information content of the
object on the left-hand side of equation (22) when it is not identically zero, we are
going to recast that object in a more geometric form.

We start by noting that, from our geometrical point of view, since D is a functional
contravariant tensor field of order two over F, its inverse D−1—which is defined by
[Dϕ]

irjr ′
[D−1

ϕ ]jr ′kr ′ ′ = δirkr ′ ′ , with δirkr ′ ′ the identity map on TϕF—is naturally a covariant

functional tensor field of order two. Hence D−1a is a covariant vector field over F, i.e.
a functional one-form. It acts on perturbations δϕ ∈ TϕF as

D−1aϕ (δϕ)≡
[
D−1aϕ

]
ir
δϕir =

[
D−1
ϕ

]
irjr ′

ajr
′

ϕ δϕir . (23)

Upon introducing δir, the Dirac delta at point r applied to the i th component of δϕ,
i.e.

δir (δϕ)≡ δϕi (r) , (24)

the one-form D−1a can be written as

D−1a=
[
D−1a

]
ir
δir . (25)

We denote by Ω1(F) the space of functional one-forms ζϕ = ζir[ϕ]δ
ir over F.

3.1.2. Functional two-forms and exterior derivative. A functional two-form γ over
F is a field of maps γϕ : (δϕ1,δϕ2) ∈ TϕF×TϕF→ γϕ(δϕ1,δϕ2) ∈ R that are bilinear

and antisymmetric for all ϕ. We denote by Ω2(F) the space of functional two-forms
over F. As promised above, we now generalize to vector-valued fields the functional
exterior derivative introduced in [14] for scalar field: the exterior derivative of a one-
form ζϕ = ζir[ϕ]δ

ir is a two-form, denoted by dζ, which acts on any pair of perturbations
δϕ1(r),δϕ2(r) ∈ TϕF as:

dζϕ (δϕ1,δϕ2)≡
d2∑

i,j=1

ˆ {
δζir [ϕ]

δϕjr ′ − δζjr ′ [ϕ]

δϕir

}
δϕjr

′

1 δϕir2 drdr
′ . (26)

The space dΩ1(F)⊂ Ω2(F) of exterior derivatives of one-forms is the vector space of exact
functional two-forms. We now defined the wedge product D1 ∧D2 of two distributions
D1,D2 : TϕF→ R as the antisymmetric bilinear map from TϕF×TϕF to R which reads

D1 ∧D2 (δϕ1,ϕ2)≡D1 (δϕ1)D2 (δϕ2)−D1 (δϕ2)D2 (δϕ1) . (27)
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This product is antisymmetric: D1 ∧D2 =−D2 ∧D1. The wedge product allows us to
re-write the exterior derivative (26) without its arguments δϕ1,δϕ2 as

dζ =
1

2

{
δζir
δϕjr ′ −

δζjr ′

δϕir

}
δjr

′ ∧ δir , (28)

which emphasizes the fact that it is a geometrical object on its own. Note that the wedge
product of Dirac deltas also allows to write any two-form γ as γϕ = γirjr ′[ϕ]δir ∧ δjr ′

,
where the γirjr ′[ϕ] play the role of components of γ along the elementary two-forms
δir ∧ δjr ′

, the latter being antisymmetric bilinear maps on each tangent space TϕF.
Just as in finite dimension, this functional exterior derivative can be extended to

differential forms of any order. In this article, in addition to the exterior derivative (26)
of one-forms, we will only need that of zero-forms, i.e. of functionals F [ϕ]. The latter
is simply defined as the differential:

dF ≡ δF
δϕir

δir . (29)

Importantly, this functional exterior derivative retains a crucial property of its finite-
dimensional counterpart: it squares to zero, i.e.

d(dF) = 0 , (30)

thanks to the functional Schwarz theorem [13] of permutation of functional derivat-
ives: δF

δϕirδϕjr ′
= δF

δϕjr ′δϕir
. In other words, exact functional one-forms are closed, as in

finite dimension. This a geometric reformulation of the fact that equation (21) implies
equation (22), as proven in [13], since the fact that equation (22) is distributional pre-
cisely means that dD−1aϕ(δϕ1,δϕ2) must vanish for all δϕ1,δϕ2. Before showing that
the reciprocal also holds, let us make a remark that will turn out to be useful in prac-
tice. Using the antisymmetry of the wedge product, the exterior derivative (28) can be
re-written as

dζ =
δζir
δϕjr ′ δ

jr ′ ∧ δir . (31)

In turn, this relates the functional derivatives of two- and one- forms through the
formula,

dζ = d
[
ζirδ

ir
]
= [dζir]∧ δir =

δζir
δϕjr ′ δ

jr ′ ∧ δir (32)

where dζir stands for the exterior derivative of ζir seen as a 0-form with i and r fixed.
Formula (32), which is the infinite-dimensional counterpart of a well-known relation in
finite dimension [31], is very convenient for practical computations. We will use this rela-
tion later on in this article to compute functional exterior derivatives (see appendices H
and I for detailed calculations).
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3.1.3. Functional Stokes theorem and Poincaré lemma. We are now in position to
show that, when F is simply-connected, the converse of equation (30) also holds, i.e.
that closed functional one-forms are exact. This represents a functional version of the
Poincaré lemma.

We show in appendix B that our functional exterior derivative satisfies a functional
version of the Stokes theorem: if S ⊂ F is a smooth oriented surface in F with smooth
boundary ∂S, then for any one-form ζ (see appendix B for details), we have

ˆ
∂S

ζ =

ˆ
S

dζ . (33)

In section 5.1.3, we will use this functional Stokes theorem to compute the entropy
production around a loop12 in F for AMB and relate it to the phenomenology of this
out-of-equilibrium model. Most importantly, equation (33) allows us to prove that,
when F is simply connected, the converse of relation (30) also holds, i.e. that a closed
functional one-form is also exact. Indeed, let us consider a one-form ζ that is closed,
i.e. dζ = 0. Then, we define the functional

F [ϕ]≡−
ˆ
C
ζ ≡−

ˆ 1

0

ζir [ϕτ ]∂τϕ
ir
τ dτ , (34)

where ϕ0 ∈ F is arbitrary, and C ≡ (ϕτ )τ∈[0,1] is an arbitrary smooth path in F connecting
ϕ0 to ϕ1 ≡ ϕ. First, the functional F [ϕ] is well defined, since picking another path
C ′ ⊂ F joining ϕ0 to ϕ in the definition (34) of F creates a difference with the right-
hand side of (34) that is equal to the integral of ζ along the loop C ∪C ′. Since F is simply
connected, there exist a surface S ⊂ F such that ∂S = C ∪C ′. Using Stokes theorem (33)
and the fact that ζ is closed, we conclude that this difference vanishes. Furthermore,
using the continuity of ζ[ϕ] we have F [ϕ+ εδϕ]'F [ϕ]− εζir[ϕ]δϕ

ir to first order in ε,
i.e. ζ =−dF , which is the functional version of the Poincaré lemma.

3.1.4. Irreversibility and vorticity. The functional Poincaré lemma implies that
equation (21) follows from equation (22). Thus the reversibility of dynamics (8) is
equivalent to

dD−1a= 0 . (35)

Indeed, if condition (35) is satisfied, a direct computation allows to show that
Pss[ϕ]≡ e−F [ϕ]/Z, where F is obtained by replacing ζ by D−1a in equation (34) and
Z ≡
´
e−F [ϕ]Dϕ is the normalizing constant, is the stationary distribution and is such

that (21) is fulfilled.
The functional two-form dD−1a associated with dynamics (8) is the central object

of this article. We will denote it by ω, i.e.

ω ≡ dD−1a , (36)

12 A loop in F corresponds to an evolution (ϕτ )τ∈[0,T ] of the field that ends up in the same state it started from, ϕ0 = ϕT .
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and, just as in [14], we will call it the (functional) vorticity two-form, or, by analogy
with its counterpart in Markov chains [32], the (functional) cycle affinity two-form.

3.1.5. Vorticity of the AMB. In order to compute the vorticity two-form (36) on a
concrete example, one first needs to rewrite the considered stochastic field dynamics
in the form (8) and, specifically, identify the operator D together with the drift a. We
already did so at the end of section 2.2 for our running example, the AMB. In particular,
using the same notation as in (25), we have D−1a=−µrδ

r. Then, the definition (26) of
the functional exterior derivative—or equivalently the convenient formula (32) – allows
to compute the vorticity two-form (36). In the case of the AMB dynamics (19) and (20),
the latter reads (see [14] or appendix C)

ω ≡ dD−1a=−d [µrδ
r] =−

ˆ
dr [2λ(ρ(r))+κ ′ (ρ(r))]∇ρ(r) · δr ∧∇δr , (37)

where κ ′ ≡ dκ
dρ and ∇δr is the gradient of the Dirac delta at r, whose action on a per-

turbation δρ ∈ TρF is ∇δr(δρ)≡−∇δρ(r). Note that the explicit expression (37) is not
entirely straightforward for a reason detailed in the introduction of section 4 (see [14]
or appendix C for two slightly different step-by-step derivations of (37)). Dynamics (19)
and (20) is then reversible iff ω is identically zero, the latter condition being fulfilled iff
2λ+κ ′ = 0. Whenever this is the case, then the chemical potential µ is the functional
derivative of the free energy F given by equation (34) with ζ ≡D−1a, which also reads

F [ρ] =

ˆ [
α

2
ρ2+

β

4
ρ4+

κ

2
|∇ρ|2

]
dr , (38)

up to an irrelevant constant. Interestingly, note that in this example that the ‘coordin-

ates’ δ[D−1a]ir
δϕjr ′

of dD−1a along the two-forms δjr
′ ∧ δir can be generalized functions13 of

r and r ′, in which case the non-local ‘basis’ δjr
′ ∧ δir can be reduced to a local one

involving Dirac deltas at r together with their derivatives at the same point. Finally,
we see that the reversibility of AMB reduces to an integrability constraint over the
chemical potential µ. This might be surprising at first sight as it does not seem to
enforce any structure of the noise, while it is known that the later should satisfy the
fluctuation-dissipation theorem at equilibrium. This constraint is in fact embedded in
the single condition (35), where the noise statistics enters through the operator D. In
the AMB dynamics (19), the FDT is enforced by the relation between the drift and
noise structure, so that D−1a reduces to µ, and reversibility of (19) amounts to the
integrability of the latter functional.

3.1.6. Other existing formalisms. To conclude this section, we emphasize that the
functional exterior calculus introduced in [14] and further developed here is by no mean
the first of its kind. Indeed, other mathematical formalisms exist (see [33, 34] and refer-
ences therein). The first advantage of the formalism presented here is its simplicity, as its

13 In the case of AMB δ[D−1a]r

δρr
′ = [2λ(ρ(r)) + κ ′(ρ(r))]∇rρ(r) ·∇r ′δ(r− r ′), up to unimportant symmetric (under r↔ r ′) terms.
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only involve functional derivatives, Dirac deltas, and the wedge product of distributions.
A second advantage is its striking analogy with the finite-dimensional exterior calcu-
lus, which allows us to straightforwardly extend known results from finite dimension,
something we will extensively do throughout this article. Finally, a major inconvenience
of the alternative formalism of jet bundles [33], which seems to be the most developed
and widespread mathematical framework for functional differential geometry, is that it
cannot handle non-local differential forms, whereas our formalism can (see section 4.4.2
and appendix I).

3.2. Two operators associated with ω

In this section, we introduce two differential operators, both associated with the two-
form ω but in different ways. They will respectively be important in the interpretation
of ω and of the results of section 4. In order to emphasize the distinction between these
operators, they will respectively be called the cycle-affinity operator and the vorticity
operator, although ω was indifferently called the vorticity two-form and the cycle-affinity
two-form.

3.2.1. The cycle-affinity operator. First, we define the cycle-affinity operator, denoted
by ω̂, as the L2-representative of ω, i.e. for all ϕ ∈ F, ω̂ϕ is such that

ωϕ (δϕ1,δϕ2) =

ˆ
Rd1

δϕ1 · ω̂ϕδϕ2dr , (39)

where the dot ‘·’ here stands for the canonical scalar product of Rd2. Using expres-
sion (26), we see that in the canonical basis of Rd2 it acts as

[ω̂ϕδϕ]j (r
′) =

d2∑
i=1

ˆ {
δ
[
D−1aϕ

]
ir

δϕjr ′ −
δ
[
D−1aϕ

]
jr ′

δϕir

}
δϕirdr . (40)

It directly follows from the skew-symmetry of ω in its arguments that ω̂ is skew-
symmetric in the L2-sense:

ω̂† =−ω̂ . (41)

In section 4.3, ω̂ will allow us to translate in the more familiar language of (skew-
symmetric) differential operators the somewhat abstract result of section 4.1 which is
formulated with functional 2-forms.

3.2.2. The vorticity operator

3.2.2.1. Definition. We now define the vorticity operator W by formally extending
to this field-theoretic context the finite-dimensional construction carried out in section
3.2.3 of our paper I [15]. In essence, it consist in considering D−1 as a Riemannian
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metric over F, which allows us to Taylor expand the vector field a in a covariant way
as:

aexpϕ(δϕ) ' τϕ→expϕ(δϕ)

[
aϕ+ ∇̃δϕaϕ

]
(42)

up to linear order, where expϕ here denotes the Riemannian exponential map14, ∇̃
the Levi-Civita covariant derivative, and τϕ→expϕ(δϕ)

the parallel transport from ϕ to

expϕ(δϕ) along the geodesic joining these two points in F. In turn, we define the vorticity

operator as the skew-symmetric part, for the metric D−1, of the linear operator ∇̃aϕ :

δϕ ∈ TϕF→ ∇̃δϕaϕ ∈ TϕF appearing in the expansion (42) of the vector field a:

Wϕδϕ≡ ∇̃A
δϕaϕ . (43)

This construction is similar to the one conducted in hydrodynamics to define the usual
vorticity of a velocity field v, albeit here in a non-Euclidean and functional context.
Hence the name chosen for W. Note that the D−1-antisymmetry of W reads

DW†D−1 =−W , (44)

or, in coordinates, Di1r1i2r2W i3r3
i2r2

[D−1]i3r3i4r4 =−W i1r1
i4r4

. This symmetry property notably
implies that the spectrum of W is purely imaginary—as is that of ω̂. Most importantly,
the vorticity operator can be shown to read (see [15]):

W i1r1
i2r2

=−1

2
Di1r1i3r3

[
δ
[
D−1a

]
i2r2

δϕi3r3
−
δ
[
D−1a

]
i3r3

δϕi2r2

]
, (45)

or, in terms of operators,

W=−1

2
Dω̂ . (46)

From equation (46) and the invertibility of D, we conclude that dynamics (8) is revers-
ible iffW= 0. This fact, together with the relation of W to the covariant expansion (42)
of a, suggests to interpret the vorticity operator as the irreversible part of dynamics (8)
at the linear level and, consequently, to use the following linear dynamics, that we call
the vortex (or vorticity) dynamics:

∂tδϕ=Wϕδϕ , (47)

as a proxy to grasp the purely irreversible behavior of dynamics (8) in the vicinity of
the state ϕ. We now further justify this approach.

14 The Riemannian exponential map expϕ sends a tangent vector δϕ at ϕ to the point expϕ(δϕ) in F reached at time one by the
geodesic that passes at time zero through ϕ with speed δϕ.
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3.2.2.2. A proxy for the TRS-breaking phenomenology. As the theory of time-
reversible stochastic time-evolution is now firmly developed, it is tempting to try to build
a theory of TRS-breaking dynamics on this foundation, i.e. to start from a stochastic
field dynamics en route to equilibrium, add a (possibly small) TRS-breaking terms to
it, and study how this additional term modifies the initial equilibrium picture. To do
so, it is natural to try to split the drift a of dynamics (8) into two parts,

a= arev + airrev , (48)

the first one, arev, ‘preserving TRS’ and the other, airrev, ‘breaking it’. This would enable
to first study the reversible limit a→ arev of dynamics (8) using tools from equilibrium
field theory. Then one could study, for instance, the deterministic dynamics ∂tϕ= airrev

to get an insight into which kinds of intrinsically irreversible behavior come into play
on top of the equilibrium limit in the full irreversible dynamics.

In the attempt of making decomposition (48) properly defined, a first natural
approach is the following: on the one hand, ‘preserving TRS’ means for arev to be
such that, as soon as airrev = 0, dynamics (8) with drift a= arev is reversible, while on
the other hand ‘breaking TRS’ means that as soon as airrev 6= 0, dynamics (8) becomes
irreversible. According to our results from section 3.1, these requirements amount to

dD−1arev = 0 , (49)

dD−1airrev = dD−1a . (50)

Unfortunately, such a decomposition suffers a severe ambiguity. Indeed the con-
straints (49) and (50) are not sufficient to uniquely determine arev and airrev since,
starting from adequate candidates (arev,airrev) to (48)–(50), and adding D times the
differential dF of a non-constant functional F [ϕ] to the first and subtracting it from

the second, i.e. (ãrev, ãirrev)≡ (arev +DdF ,airrev −DdF), yields another distinct, and
equally-valid, pair of candidates.

To remedy this issue, one can choose arev and airrev to be respectively the symmetric
and antisymmetric part of a under time-reversal, which we here denote by Sa and
Aa. Once again, the conventions introduced in section 2 allow us to straightforwardly
generalize the known expressions of S,Aa from finite dimension (see for instance our
paper I [15]) to field theory, yielding

arev ≡ Sa=Dd lnPss , (51)

airrev ≡ Aa= a−Dd lnPss , (52)

where Pss is the stationary probability density of dynamics (8). Clearly, this choice (51)
and (52) provide a unique decomposition (48) while satisfying the necessary condi-
tions (49) and (50). The problem now is that, since the explicit expression of Pss is gen-
erically unknown, those of arev and airrev are also unknown, thus making the choice (51)
and (52) generally useless for practical purposes.
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Another possibility to lift the degeneracy left by the constraints (49) and (50), is to
perform a functional Hodge decomposition of the one form D−1a. Since F is assumed to
be simply connected, this decomposition should15 read D−1a=αex+αcoex, where αex

and αcoex are exact and co-exact one-forms16, respectively. The resulting decomposi-
tion (48) is such that

arev ≡Dαex , (53)

airrev ≡Dαcoex , (54)

and again satisfies the necessary conditions (49) and (50). Unfortunately, we are not
aware of any explicit formulas to perform such a decomposition in the context of func-
tional one-forms. Thus this alternative to (51) and (52) seems to suffer a similar intract-
ability issue.

In this article, we circumvent this ambiguity of the decomposition (48) as follows. To
get an insight into the reversible part of the dynamics, we suggest to choose parameters
in a given dynamics (8) in such a way that dD−1a= 0. For instance for AMB, this would
amount to choosing λ and κ such that 2λ+κ ′ = 0. In general, the resulting equilibrium
limit will be not unique, but if the hydrodynamics under study is simple enough, we do
not expect the corresponding phenomenologies to differ too much from one equilibrium
limit to the other. In practice, we will not systematically use this proxy of the ‘reversible
part’ of the dynamics, but rather focus on getting an insight into the ‘irreversible part’
of the phenomenology. We will do this by studying the vorticity dynamics (47). The
right-hand side of equation (47) is a ‘linear approximation of the irreversible drift of (8)’
in the sense that it is not the full linearization of the drift,

δa

δϕ
δϕ=Wδϕ+

[
δa

δϕ
−W

]
δϕ , (55)

but rather only the part of it that is responsible for TRS breakdown: the anti-symmetric
part of the covariant expansion of a for the metric D−1, Wδϕ. The advantages of this
approach are that it is often amenable to analytical calculation (as we will see later
in section 4) and that it does not suffer the ambiguity left by (49) and (50). Indeed,
using (46), (39) and (52), for any airrev satisfying (48)–(50), we have

Wδϕ= − 1

2
Dω̂δϕ

= − 1

2
Dd
[
D−1a

]
(·,δϕ)

= − 1

2
Dd
[
D−1airrev

]
(·,δϕ) ,

15 As far as we now, this remains unproven for functional spaces.
16 This means that there exist a functional F and a functional antisymmetric contravariant tensor of order two Airjr ′ such that

αex = dF and αcoex
ir =− δAirjr

′

δϕjr
′ (the latter formula being valid in orthonormal coordinate systems in both Rd1 and Rd2 ).

https://doi.org/10.1088/1742-5468/add0a2 21

https://doi.org/10.1088/1742-5468/add0a2


Geometric theory of (extended) time-reversal symmetries in stochastic processes: II. Field theory

J.S
tat.

M
ech.(2025)

053204

where, for any functional two-form γ and vector field δϕ, we denote by γ(·,δϕ) the
one-form δϕ0 7→ γ(δϕ0,ϕ). Considering the vorticity dynamics (47) lifts the ambiguity
discussed above because the set of gauge choices authorized by the requirements (48)–
(50) is precisely that of exact one-forms and thus coincides with the kernel of the exterior
derivative: d[D−1(airrev −DdF)] = dD−1airrev.

A delicate question that arises in our linear approach is the choice of the base-point
ϕ in equation (47). In the spirit of the approach advocated below equation (48), one
could choose ϕ as the average profile of the equilibrium limit. Another possibility, if
the stationary probability of the full dynamics (8) is concentrated in the vicinity of
a profile ϕss, is to choose the latter as the base-point in equation (47). In this case
indeed, dynamics (8) in steady-state fluctuates in the vicinity of ϕss and the linear
approx (47) with base-point ϕss describes the irreversible behavior of these fluctuations.
The effectiveness of our approach in such a case is exemplified below using AMB.

Nevertheless, as we will see in section 4.4, our approach is relevant beyond this
peculiar situation where the stationary measure is concentrated in the vicinity of a
certain profile. In this article in particular, the choice of profile ϕ in the vicinity of
which dynamics (47) is analyzed, will not be prominent, as we will study the generic
dynamics (8) in two limit-regimes (described below) in which the exact structure of ϕ
is not crucial, but only allows for a more precise analysis.

3.2.2.3. Connection of W with the Stratonovitch-averaged dynamics and instantons.
Directly generalizing a finite-dimensional result [15], the operator W interestingly

plays a similar role for the Stratonovitch-averaged dynamics of (8), which reads ∂tϕ=
vss[ϕ], with vss ≡ Jss/Pss = a−Dd lnPss =

Aa, i.e. it is the D−1-antisymmetric part of
the covariant linear expansion of vss.

Besides, it worth noting that the vorticity operator W generates the irreversible
component of the instanton dynamics associated with (8). Indeed, the path-probability
density of dynamics (8), conditioned to a given initial state ϕ0, satisfies

P
[
(ϕt)t∈T

]
∝ e−S[(ϕt)t∈T]. (56)

There exist several approaches to build a covariant action S (see [35] and references
therein). Again generalizing results from finite dimension, the approaches of DeWitt [36]
and Graham [37] in particular give actions that read

S
[
(ϕt)t∈T

]
=

ˆ T

0

[
1

4
Dirjr ′

(
ϕ̇ir− airλ

)(
ϕ̇jr

′ − ajr
′

λ

)
+

1

2
divλ (aλ)+

c

2
R

]
, (57)

where the dot stands for partial differentiation with respect to time, c= 1/3 and 1/6
in the DeWitt and Graham approaches respectively, λ is now the volume measure
on F associated with the Riemannian metric D−1, and divλ = det(D) δ

δϕir det(D
−1) the

corresponding divergence operator. Extremizing the action then leads to the instanton
dynamics:

ϕ̈i1r1 +Γi1r1i2r2i3r3
ϕ̇i2r2ϕ̇i3r3 =Di1r1i2r2

δV

δϕi2r2
+2W i1r1

i2r2
ϕ̇i2r2 , (58)
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where the Γi1r1i2r2i3r3
are the Christoffel symbols associated to the D−1-Levi-Civita connec-

tion on F, and the functional V [ϕ] reads

V [ϕ]≡ 1

2
aλ ·D−1aλ+ divλ (aλ)+ cR . (59)

We see that reversing the time variable in the instanton equation (58) flips the sign of
the last term on the right-hand side. In other word, this last term, which is generated by
twice the vorticity operator W, is the deterministically time-antisymmetric part of the
instanton dynamics (58) associated with dynamics (8). In equation (58), 2W plays the
role of a (cross product by a) magnetic field whose infinite-dimensional vector potential
is D−1a (for the geometry given by D−1). Interestingly, the irreversible part of the
instanton dynamics, is not approximated at the linear level by (twice) the flow of W,
but exactly coincides with it.

3.2.2.4. Two limit-regimes amenable to analytical predictions. Before turning to the
example of AMB, let us first discuss the generic dynamics (47). We here only consider
the case where Wϕ is a local differential operator for all ϕ, in which case it generically
reads

Wϕ =
∑
K

WK (r, [ϕ])
∂|K|

∂rK
, (60)

where K = (k1, . . . ,kd1) is a multi-index of natural numbers, with the conventions
∑

K ≡∑
k1,...,kd1

(each sum being finite) and

∂|K|

∂rK
≡ ∂k1+···+kd1

∂rk11 . . .∂r
kd1
d1

. (61)

In equation (60), WK are d2× d2 matrices that, for a given ϕ, vary with r on a typical
spatial scale ℓW , which is that of typical variations in the field ϕ itself, so long as
the original dynamics (8) is translation-invariant. Dynamics (47) has no reason to be
solvable explicitly in general. However, there are two interesting limit regimes where the
solution of (47) can be approximated. The first one corresponds to the case where the
chosen perturbation δϕ varies on a scale ℓδϕ that is much larger than ℓW , i.e. ℓδϕ � ℓW .
In this case, the dominant term in Wϕδϕ is the zero-order one and the dynamics can

be approximated by ∂tδϕ(r, t)'W(0,...,0)(r, [ϕ])δϕ(r, t) and hence explicitly solved. Note

that, as soon as W(0,...,0) is not purely antisymmetric, then δϕ will tend to increase on
some spatial domains and decrease on others in such a way that, after some time, ℓδϕ ∼
ℓW and the approximation will no longer be valid. On the other hand, if δϕ is now such
that ℓδϕ � ℓW , the dominant terms in Wϕδϕ are those of maximal order in derivation,

and the corresponding matrices W(k1,...,kd1 ) can be considered piece-wise constant on the
spatial domain. Consequently, on each of these subdomains, the resulting approximation
of W is independent of r and thus amenable to Fourier analysis. The existence of these
two limit regimes—that correspond to diagonal approximations of (47) in real and
Fourier space, respectively—will be exploited several times in the rest of this article.
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3.2.2.5. Vorticity operator and phenomenology: the example of AMB. In [14], the vor-
ticity two-form of AMB was used to unveil the leading-order (in weak noise amplitude)
phenomenon that breaks TRS in the phase separated state. The latter corresponds to
the permanent excitation of anisotropic modes propagating at the liquid-gas interface,
either from the liquid to the gas, or the other way around, depending on the sign of
2λ+κ ′. This was shown in [14] through the intermediate step of the analysis, via ω, of
the structure of the stationary probability current.

Interestingly, this phenomenology can also be uncovered—and even specified—by the
dynamics (47) generated by the vorticity operator. In the case of the AMB dynamics (19)
and (20), using equations (37), (39) and (46), the latter is readily shown to act as (see
appendix C for the detailed derivation):

Wρδρ=
1

2
M∆{(2λ+κ ′)∇ρ ·∇δρ+∇· [δρ(2λ+κ ′)∇ρ]} , (62)

where δρ is a perturbation around a given profile ρ. In the vicinity of the average
phase-separated profile ρss, we start by focusing on the second of the two limit-regimes
mentioned above, i.e. we consider a perturbation δρ that varies on much smaller spatial
scales than ρss does. The action of Wρss on δρ can then be approximated as:

Wρssδρ'M (2λ+κ ′)∇ρss ·∇∆δρ . (63)

First, we see that, at least at this linear level, the effect of activity is localized at the
liquid-gas interface, where ∇ρss 6= 0, as reported in [14, 17]. Further, equations (47)
and (63) recover the aforementioned propagating-wave phenomenology uncovered
in [14]. This is most readily seen in dimension d1=1 by injecting a harmonic per-
turbation δρ∝ ei(wt−kx) in equations (47)–(63), leading to the dispersion relation:

w =M (2λ+κ ′)(∂xρss)k
3 . (64)

From equation (64), we indeed recover the fact that waves propagate from the gas to
the liquid if 2λ+κ ′ > 0, and the other way around if 2λ+κ ′ < 0, as predicted and
measured in [14]. But it is worth noting that this method—of analyzing the leading-
order irreversible phenomenon through the vorticity operator – goes further than the
one used in [14] as it also predicts the dispersion relation (64) of these waves.

Let us now examine the opposite limit-regime, i.e. when δρ varies on much larger
scales than ρss does. Assuming 2λ+κ ′ constant for simplicity, the linear dynamics (47)
becomes:

∂tδρ= δρM (2λ+κ ′)∆2ρss , (65)

the solution of which reads

δρ(x, t) = δρ(0,x)exp
[
M (2λ+κ ′)∆2ρss (x)

]
. (66)

Consequently, if 2λ+κ ′ > 0 for instance, δρ will tend to accumulate on the liquid side of
the interface and be depleted on the gaseous side, thus ‘compressing’ the liquid droplet
(see figure 1). Conversely, if 2λ+κ ′ < 0, the liquid droplet will tend to spread. Of course,
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Figure 1. A schematic picture of the left boundary of the phase-separated, steady-
state, average profile ρss of AMB and its derivative of order four. We see that the
fourth derivative d4

dx4ρss, which coincides with ∆2ρss is d1=1 dimension, displays
a positive (respectively negative) peak on the liquid (respectively gaseous) side of
the interface. This justifies the qualitative interpretation of equation (66) above.
As this is only for illustrative purpose we took the function tanh(x) instead of
a real estimate of ρss(x) (the two curves in fact becoming identical in the limit
2λ+κ ′ → 0).

after some time, the typical spatial scale of δρ will no longer be much greater than that
of ρss and equation (65) will cease to be a correct approximation, hence preventing
δρ from blowing up at long times. Moreover, in the full dynamics (19) and (20), the
counterpart of the term of the right-hand side of equation (65), which pumps mass from
or towards the droplet, will be counterbalanced by a reversible term that stabilizes the
stationary profile. These predictions of the influence of activity on the droplet size are
in accordance with the binodal shift, caused by activity, in AMB [14, 16].

We conclude this section by emphasizing that, although we used a linear equation to
conduct our analysis, the naive linearization of dynamics (19) and (20) alone (in which
reversible and irreversible ingredients are entangled) could not have been directly used
to predict the leading order irreversible phenomenon around a phase-separated profile
as we just did.

4. From explicit reversibility condition(s) to classification of nonequilibrium field
theories

As announced in the introduction, the integrability condition (1) for a functional one-
form ζ(r, [ϕ]), or even its more geometric version dζ = 0, might not be straightforward
to use when looking for the concrete reversibility condition(s) of a given field dynamics.
This issue was not visible on the AMB example reported in section 3.1 because we
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directly gave a convenient expression (37) of its vorticity two-form ω ≡ dD−1a. Indeed,
the explicit calculation of ω, detailed in [14], first leads to the expression

ω =−
ˆ

dr2λ∇ρ · δr ∧∇δr−
ˆ

drκδr ∧∆δr . (67)

At this stage, it would be wrong to conclude that, for ω to vanish, λ(ρ) and κ(ρ)
both need to be identically zero. This is because the elementary two-forms δr ∧∇δr
and δr ∧∆δr are not independent17 as they differ by a total derivative. Indeed, for an
arbitrary pair of fluctuations δρ1,δρ2,

δr ∧∆δr (δρ1,δρ2) ≡ δρr1∆δρ
r
2− δρr2∆δρ

r
1

=∇· [δρr1∇δρr2− δρr2∇δρr1]
= −∇ · [δr ∧∇δr (δρ1,δρ2)] ,

where the minus sign in the last expression comes from the sign convention of the
gradient of the Dirac delta: ∇δr(δρ) =−∇δρr. This relation, that we may summarize
as

δr ∧∆δr =−∇ · [δr ∧∇δr] , (68)

can then be injected into equation (67). After integrating by parts the factorized gradient
in the resulting equation, one gets expression (37) of the vorticity two form, from which
one can easily show that ω = 0 (i.e. ωρ = 0 for all ρ) iff 2λ+κ ′ = 0, which is the correct
integrability condition for D−1a=−µ and hence the right reversibility condition for
AMB.

The example of AMB shows that, at least for a field dynamics (8) whose one-form
ζ ≡D−1a is expressed as a gradient expansion in ϕ, one needs to express the vorticity
ω as a sum of integrals against elementary two-forms that are independent—in the
appropriate sense—in order to determine the concrete reversibility condition(s). To be
even more systematic, we would ideally like to determine a basis of 2-forms, i.e. a family
of independent elementary two-forms on which dζ can always be developed, whatever
ζ(r, [ϕ]). In section 4.1, we completely solve this problem in d1=1 spatial dimension
for the case of a one-form ζ(x, [ϕ]) that is local in ϕ. We then partially extend in 4.2
our result to higher dimensions by determining a free family of two-forms. The latter is
incomplete in the sense that it does not span the entire space of vorticity two-forms of
arbitrary field dynamics. However this family turns out to be sufficient in many practical
cases.

To shed light on our notion of a basis of two-forms, we translate it in the more
common language of differential operators in section 4.3. More precisely, we use the
notion of the affinity operator (39) introduced in section 3.2 to show that this basis
of functional 2-forms is in one-to-one correspondence with a basis of antisymmetric
operators.

17 What we here mean by ‘independent’ will be made more precise in section 4.1.
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To get an insight into the phenomenology associated to each basis element, we then
analyze in section 4.4 the linear dynamics (47) generated by each respective vorticity
operator. This approach will show that these elementary two-forms can be classified
into three subfamilies whose respective members have similar phenomenologies. For
each of these subfamilies, we also give concrete examples whose known phenomenology
are in good agreement with our analysis based on the flow of their vorticity operator as
captured by (47).

Finally, in section 4.5, we summarize our results, discuss their limitations, and elab-
orate on their possible extension to more general situations.

4.1. A basis of 2-forms in one spatial dimension

4.1.1. Local one-forms and two-forms. At the end of section 2, we defined a notion
of locality for a map µ(r, [ϕ]) that is both a function of r and a functional of ϕ. We
now extend this notion for one- and two- forms. From now on, a functional one-form
ζϕ = ζir[ϕ]δ

ir is said to be a local one-form when its coordinate function(al)s ζir[ϕ] are

local maps. We denote by Ω1
loc(F) the space of local one-forms over F. We define the

notion of local two-forms in a slightly different way: a two-form γϕ = γirjr ′[ϕ]δir ∧ δjr ′

is a local two-form when it can be written as

γ =
∑
K

γ
(K)
ijr [ϕ]δir ∧ ∂|K|

∂rK
δjr , (69)

where the γ
(K)
ijr [ϕ] depend smoothly on ϕ and r, but do not have to be local as maps18

of the variables r and ϕ. In other words, γ is local two-form whenever γϕ(δϕ1,δϕ2)
is an integral over r of a function that depends only on the value of each δϕi and its
derivatives (up to a finite order) at r, whatever the functional dependence of γϕ with
respect to ϕ. In equation (69), we use the same notations as in equation (60) and we
implicitly sum over i,j and integrate over r (we integrate only once, despite r appearing

twice as an upper index). Note that the relation between γirjr ′ and γ
(K)
ijr reads

γirjr ′ =
∑
K

γ
(K)
ijr (−1)|K| ∂

|K|

∂r ′K
δ (r− r ′) . (70)

We denote by Ω2
loc(F) the space of local two-forms over F.

Before turning to the space of local exact two-forms dΩ1
loc(F), to which the vorticity

ω belongs when D−1a is local, we first study in detail the space of local two-forms
Ω2

loc(F), the latter space containing the former:

dΩ1
loc (F)⊂ Ω2

loc (F) . (71)

18 We could alternatively require the γ
(K)
ijr [ϕ] to be local as maps. All the results presented in this article would still be valid. But

as this constraint is not mandatory for our study, we lift it from the definition of local two-forms to make our results slightly more
general.
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4.1.2. A basis of the space of local two-forms Ω2
loc(F). Until the end of section 4.1, we

focus on the case of d1=1 spatial dimension, where a local two-form generically reads

γ =

q∑
k=0

γ
(k)
ij x [ϕ]δ

ix ∧ ∂kδj x , (72)

with the abbreviation ∂k ≡ dk

dxk is used from now on to lighten notations. This expres-
sion of a generic local one-form γ suffers a redundancy issue as it involves, for instance,
the elementary two-forms δix ∧ ∂2δix, which can be ‘decomposed’ along δix ∧ ∂δix upon
factorizing a spatial derivative (68) and integrating by parts, as explained in the intro-
duction of section 4. We now solve this redundancy problem by determining a family of
elementary two-forms, that are independent of each other in the appropriate sense, and
on which any local two-form can be uniquely decomposed. We do this by first showing
in appendix E that (the d1=1 version of) relation (68) generalizes as follows:

δi ∧ ∂2ℓδj + δj ∧ ∂2ℓδi =−
ℓ−1∑
k=0

b2ℓ2k+1∂
2ℓ−2k−1
x

[
δi ∧ ∂2k+1δj + δj ∧ ∂2k+1δi

]
, (73)

δi ∧ ∂2ℓ+1δj − δj ∧ ∂2ℓ+1δi =−
ℓ∑

k=0

c2ℓ+1
2k ∂2ℓ−2k+1

x

[
δi ∧ ∂2kδj − δj ∧ ∂2kδi

]
, (74)

the coefficients b2ℓ2k+1 and c2ℓ+1
2k being given by equations (229)–(231) of appendix D.

In turn, injecting these relations back into equation (72), integrating by parts several
times, and rearranging the terms (see appendix E for details) allows us to prove that
the generic local two-form γ can be re-written as

γ =

bq/2c∑
ℓ=0

∑
1⩽i<j⩽d2

ˆ
dxα

(ℓ)
ij (x, [ϕ])

(
δix ∧ ∂2ℓδjx− δjx ∧ ∂2ℓδix

)
+

b(q−1)/2c∑
ℓ=0

 ∑
1⩽i<j⩽d2

ˆ
dxβ

(ℓ)
ij (x, [ϕ])

(
δix ∧ ∂2ℓ+1δjx+ δjx ∧ ∂2ℓ+1δix

)
+

d2∑
i=1

ˆ
dxβ

(ℓ)
ii (x, [ϕ])δix ∧ ∂2ℓ+1δix

}
, (75)

where the ‘coordinate functions’ α
(ℓ)
ij (x, [ϕ]) and β

(ℓ)
ij (x, [ϕ]) respectively read

α
(ℓ)
ij = Aγ

(2ℓ)
ij +

b(q−1)/2c∑
k=ℓ

c2k+1
2ℓ ∂2k+1−2ℓ

x

[
Aγ

(2k+1)
ij

]
(76)

and
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β
(ℓ)
ij = Sγ

(2ℓ+1)
ij +

bq/2c∑
k=ℓ+1

b2k2ℓ+1∂
2k−2ℓ−1
x

[
Sγ

(2k)
ij

]
, (77)

the matrices S/Aγ(k) being respectively the symmetric and antisymmetric parts of γ(k),

i.e. S/Aγ
(k)
ij ≡ (γ

(k)
ij ± γ

(k)
ji )/2. This result implies that the family of functional 2-forms

given by

(
[
δix ∧ ∂2ℓδjx− δjx ∧ ∂2ℓδix

]︸ ︷︷ ︸
antisymmetric

,
[
δix ∧ ∂2ℓ+1δjx+ δjx ∧ ∂2ℓ+1δix

]
,δix ∧ ∂2ℓ+1δix︸ ︷︷ ︸

symmetric

)1⩽i<j⩽d2,ℓ∈N,x∈R (78)

is generative for the space Ω2
loc(F), the ‘linear combinations’ over this family consisting

in summing and integrating over its discrete and continuous indices, respectively. Under
equation (78), we attributed names to subfamilies whose meaning will be justified soon.

Importantly, in addition to its generative aspect, we further prove in appendix E.2
that the family (78) is also free in the sense that

γ = 0⇔
[(
α
(ℓ)
ij

)
1⩽i<j⩽d2,ℓ∈N

= 0 and
(
β
(ℓ)
ij

)
1⩽i⩽j⩽d2,ℓ∈N

= 0

]
. (79)

This family can thus be seen a basis of the space of two-forms Ω2
loc. In other words, in

d1=1 spatial dimension, a local two-form γ ∈ Ω2
loc can be uniquely decomposed over

the family (78).

Note that equations (81) and (82) obey the symmetries α
(ℓ)
ij =−α(ℓ)

ji and β
(ℓ)
ij = β

(ℓ)
ji ,

respectively. This suggests reformulating the rather lengthy expression (75) of γ in a
more compact form, albeit at the price of making the decomposition over the basis (78)
less visible:

γ =

bq/2c∑
ℓ=0

ˆ
dxα(ℓ) (x, [ϕ]) : δx ∧ ∂2ℓδx+

b(q−1)/2c∑
ℓ=0

ˆ
dxβ(ℓ) (x, [ϕ]) : δx ∧ ∂2ℓ+1δx ,

where ‘:’ represents the full tensor contraction between the antisymmetric matrix

α(ℓ) ≡ (α
(ℓ)
ij )i,j=1...d2 (respectively the symmetric matrix β(ℓ) ≡ (β

(ℓ)
ij )i,j=1...d2) and the

Rd2 ⊗Rd2-valued 2-forms [δx ∧ ∂kδx]ij ≡ δix ∧ ∂kδjx. The symmetry properties of the
matrices α and β justifies the names given in (78) to each of the two subfamilies:
the space spanned by the antisymmetric (respectively symmetric) family of elementary
2-forms is obtained by contracting δx ∧ ∂2ℓδx (respectively δx ∧ ∂2ℓ+1δx) with antisym-
metric matrices (respectively symmetric matrices).
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4.1.3. Coordinates of an exact local two-form. Let us now consider a local 1-form
ζϕ = ζix[ϕ]δ

ix where ζix[ϕ] = ζi (ϕ(x),∂xϕ(x), . . . ,∂
q
xϕ(x)) for a given integer q. Using

formula (32), the functional exterior derivative of ζ reads:

dζ =
δζix
δϕj y

δj y ∧ δix

=

q∑
k=0

∂ζix
∂ (∂kϕj)

(−1)k ∂ky δ (x− y)δj y ∧ δix

=

q∑
k=0

(−1)k+1 ∂ζix
∂ (∂kϕj)

δix ∧ ∂kδjx .

where the last equality is straightforwardly obtained by evaluating each side on a pair
of perturbations δϕ1,δϕ2. As announced in (71), dζ is a local two-form, hence we can
decompose it on the basis (78). When compared to the generic local two-form γ, using
equation (72), we have the relation

γ
(k)
ij ↔ (−1)k+1 ∂ζix

∂ (∂kϕj)
. (80)

Using this relation, together with equations (76) and (77), we deduce the ‘coordinate

functions’ α
(ℓ)
ij (x, [ϕ]) and β

(ℓ)
ij (x, [ϕ]) of dζ, which respectively read

α
(ℓ)
ij =

1

2

 ∂ζj

∂ (∂2ℓϕi)
− ∂ζi

∂ (∂2ℓϕj)
−

b(q−1)/2c∑
k=ℓ

c2k+1
2ℓ ∂2k+1−2ℓ

x

(
∂ζj

∂ (∂2k+1ϕi)
− ∂ζi

∂ (∂2k+1ϕj)

) (81)

and

β
(ℓ)
ij =

1

2

 ∂ζj

∂ (∂2ℓ+1ϕi)
+

∂ζi

∂ (∂2ℓ+1ϕj)
−

bq/2c∑
k=ℓ+1

b2k2ℓ+1∂
2k−2ℓ−1
x

(
∂ζj

∂ (∂2kϕi)
+

∂ζi

∂ (∂2kϕj)

) . (82)

When ζ is the one-form D−1a associated to dynamics (8), this allows reformulating the
reversibility (35) in an explicit, readily applicable, form:

ω ≡ dD−1a= 0⇔
[(
α
(ℓ)
ij

)
1⩽i<j⩽d2,ℓ∈N

= 0 and
(
β
(ℓ)
ij

)
1⩽i⩽j⩽d2,ℓ∈N

= 0

]
, (83)

where the α(ℓ) and β(ℓ) are respectively given by (81) and (82) with ζ ≡D−1a.
To illustrate this result, let us show that it directly gives the convenient expres-

sion (37) of the vorticity of the one-dimensional AMB and thus, in particular, its revers-
ibility condition as well. Since the density field ρ is scalar valued, the basis (78) reduces
to the subfamily (δx ∧ ∂2ℓ+1δx)ℓ∈N,x∈R. Further, ζ =D−1a=−µ is a local functional of ρ
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of order q =2. Hence the only possible term in the vorticity two-form is
´
β
(0)
11 δ

x ∧ ∂xδx.
A direct application of formula (82) then gives

β
(0)
11 =

∂ζ

∂ (∂xρ)
− b21∂x

∂ζ

∂ (∂2xρ)
=− [2λ∂xρ− ∂x (−κ)] =−(2λ+κ ′)∂xρ , (84)

where we used formulas (229) and (231) to get that b21 = 1. Thus, as expected, we recover
the (one-dimensional version of the) convenient expression of the AMB vorticity (37),
from which we can directly conclude that reversibility is equivalent to 2λ+κ ′ = 0.

4.1.4. Further decomposition of the space of local two-forms. Our partitioning of the
basis (78) between the antisymmetric and symmetric subfamilies already provides a
decomposition of Ω2

loc(F). But, as we will see in section 4.4.2, it is physically meaningful
to further decompose the symmetric subfamily as follows. In general, the field ϕ is
not a ‘true’ vector field19 but is rather made out of n distinct physical fields (of mass
density and polarity for instance) stacked together, i.e. ϕ= (ϕ(1), . . . ,ϕ(n))

>. The set of

coordinate indices I = {1, . . . ,d2} of ϕ= (ϕi)i∈I can then be partitioned as I = ∪nk=1Ik
, where Ik is the set indexing the coordinates of ϕ(k). In turn, this allows partitioning
of the symmetric family into two subfamilies. In the first one, that we call the self-
symmetric family, the coordinate indices i and j appearing in the expression of a given
elementary two-form belong to a common subset Ik:([

δix ∧ ∂2ℓ+1δjx+ δjx ∧ ∂2ℓ+1δix
]
,δix ∧ ∂2ℓ+1δix

)
I(i)=I(j),1⩽i<j⩽d2,ℓ∈N,x∈R . (85)

where I (i) denotes the subset Ik of I to which a given index i belongs. In the second
one, that we call the inter-symmetric family, i and j belong to two different subset of
I : (

δix ∧ ∂2ℓ+1δjx+ δjx ∧ ∂2ℓ+1δix
)
I(i) 6=I(j),1⩽i<j⩽d2,ℓ∈N,x∈R . (86)

The components of γ along the self-symmetric subfamily then correspond to the diag-
onal blocks20 of each β(ℓ) in (80), while those along the inter-symmetric family are given

by all the other components of each β(ℓ). Physically, we will see in section 4.4.2 that
the elements of the inter-symmetric family in the vorticity ω of dynamics (8) are due
to TRS-breaking interactions between distinct fields ϕ(i) 6= ϕ(j), while any element of
the self-symmetric family originates from a field ϕ(i) whose evolution is irreversible on
its own.

At the level of vector spaces, our partitioning of the basis (78) can thus be formulated
as the decomposition

Ω2
loc (F) =A⊕Sself ⊕Sinter , (87)

19 If ϕ is a true vector field, then ϕ(r) is a vector, a geometrical object on its own that can be equally described in any basis. On
the other hand, if for instance the field consists in a density field ρ and a polarity field p stacked together, ϕ = (ρ,p), then all
the possible bases of R4 are not equivalent to describe ϕ(r): those mixing the first coordinate with the others are not physically
meaningful.
20 The n diagonal blocks of β(ℓ) are (β

(ℓ)
ij )i,j∈Ik , k = 1, . . . ,n.
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where A, Sself , and Sinter are respectively the antisymmetric, self-symmetric and inter-
symmetric subspaces, each one being the linear span21 of the subfamily of (78) that
bears the corresponding name.

4.2. Partial extension to higher spatial dimension d 1

We now discuss how the results of section 4.1 generalize, at least partially, to higher
spatial dimension d1 > 1. Let us consider the family of two-forms obtained by grouping
together d1 copies22 of the family (78) where each derivative23 ∂x is replaced by ∂rk in
the kth copy, i.e.([

δir ∧ ∂2nrk δ
jr− δjr ∧ ∂2nrk δ

ir
]
,
[
δir ∧ ∂2ℓ+1

rk δjr+ δjr ∧ ∂2ℓ+1
rk δir

]
,

δir ∧ ∂2ℓ+1
rk δir

)
1⩽k⩽d1,1⩽i<j⩽d2,n∈N*,ℓ∈N,x∈Rd1

. (88)

This family turns out to be free in the same sense as its one dimensional counterpart (78)
(see the end of appendix E.2). Further, it can be shown24 that it is generative for exterior
derivatives of one-forms ζ(r, [ϕ]) that locally depend on ϕ but not through any cross
derivative, i.e. which are of the form

ζ (r, [ϕ]) = ζ
(
ϕ(r) ,

{
∂rkϕ(r) , . . .,∂q

rk
ϕ(r)

}
k=1,...,d1

)
. (89)

For this particular subspace of exterior derivatives of one-forms, the family (88) is
thus a basis. However, the family (88) can generate neither the exterior derivative of

local one-forms whose dependence in ϕ involve cross derivatives, like e.g. ∂2ϕ(r)
∂r1∂r2 , nor

consequently the whole space of local two-forms. The family (88) hence generalizes (78)
and its properties only partially to dimensions d1 > 1.

We can extend the partition of (78) into antisymmetric, self-, and inter- symmetric
subfamilies to (88), by the same procedure25 through which we defined (88) from (78),
and still denote the corresponding subspace by A, Sself , and Sinter, respectively. In d1 > 1
spatial dimension, the decomposition (87) thus generalizes to

Ω2
loc (F) =A⊕Sself ⊕Sinter⊕C . (90)

Here C is a complement of A⊕Sself ⊕Sinter in Ω2
loc(F) and hence allows to decompose,

in particular, the exterior derivative of any local one-form ζ that depends on cross-
derivatives of ϕ. Finding a basis of a suitable complement C is an interesting challenge
that is left for future work.

Despite its incompleteness in generic situations, the family (88) is sufficient to decom-
pose the vorticity two-form of many celebrated physical models. For instance, this is the

21 The linear span of a given family is to be understood here as integrating and summing (with respect to discrete and continuous
indices, respectively) the elements of this family against function(als) fij(x, [ϕ]).
22 We exclude from the additional copies the elements that are of order n =0 in derivation.
23 Recall that, to lighten notations in the previous section, we denoted the distribution ∂kxδ

ix by ∂kδix.
24 Indeed, at each step of section 4.1, this amounts to replace all the spatial derivatives by ∂

∂rn
, and to sum from n =1 to d1.

25 For instance, the antisymmetric subfamily in dimension d1 > 1 is obtained by gathering the d1 ‘copies’ of the one dimensional
antisymmetric family, one for each direction of space rk.

https://doi.org/10.1088/1742-5468/add0a2 32

https://doi.org/10.1088/1742-5468/add0a2


Geometric theory of (extended) time-reversal symmetries in stochastic processes: II. Field theory

J.S
tat.

M
ech.(2025)

053204

case for AMB in arbitrary spatial dimension d1 since its one-form D−1a=−µ, where
µ(r, [ϕ]) is given by equation (20), depends locally on ρ but not through any cross deriv-
ative. The resulting vorticity ω =−dµ, given by equation (37), is generated by the basis
elements (δr ∧ ∂rkδr)k=1,...,d1 of the self-symmetric family. Another example is given by
the KPZ equation, whose vorticity is the same as that of AMB [14].

After this short detour through higher spatial dimensions, we will stick to the d1=1
case in the rest of section 4 for simplicity, keeping in mind that most of the following
results can be generalized from the family (78)–(88).

4.3. Relation between functional two-forms and skew-symmetric differential operators

We have seen in section 3.1 that the question of the reversibility of dynamics (8) is geo-
metrically a question of exactness (or integrability) of the functional one-form D−1a.
Consequently, the language of functional differential forms appears to be, mathemat-
ically, the most natural one to tackle it. Nevertheless, functional differential forms are
not commonly used in physics and even less the corresponding formalism introduced in
this article. Hence, before turning to the study of the phenomenology associated to each
element of the basis (78), we give here an alternative description in the more common
language of differential operators.

To this end, let us start by extending to the whole space Ω2(F) the map ‘hat ’, defined
in section 3.2, that associates to a vorticity two-form ω ∈ dΩ1(F) the corresponding
cycle affinity operator ω̂. For any two-form γ ∈ Ω2(F), the corresponding ‘cycle-affinity
operator’ γ̂ ≡ hat(γ) is obtained by replacing ω and ω̂ in definition (39) respectively
by γ and γ̂. We now restrict our attention to two-forms γ that are local, γ ∈ Ω2

loc(F).
Then, injecting expression (80) into definition (39) and performing several integrations
by parts, we get:

[γ̂ (δϕ)]i =

bq/2c∑
ℓ=0

d2∑
j=1

[
α
(ℓ)
ij ∂

2ℓ
x δϕ

j + ∂2ℓx

(
α
(ℓ)
ij δϕ

j
)]

−
b(q−1)/2c∑

ℓ=0

d2∑
j=1

[
β
(ℓ)
ij ∂

2ℓ+1
x δϕj + ∂2ℓ+1

x

(
β
(ℓ)
ij δϕ

j
)]

, (91)

or, in terms of operators:

γ̂ =

bq/2c∑
ℓ=0

[
α(ℓ)∂2ℓx + ∂2ℓx α

(ℓ)
]
−

b(q−1)/2c∑
ℓ=0

[
β(ℓ)∂2ℓ+1

x + ∂2ℓ+1
x β(ℓ)

]
. (92)

Each differential operator in the first (respectively second) sum on the right-hand of
equation (92) is the cycle affinity operator associated to a two-form that belongs to
the antisymmetric (respectively symmetric) subspace. Moreover, we see that each one
is, up to a factor 1/2, the skew-symmetric part of an operator that applies an even-
(respectively odd-) degree derivative and multiplies by a skew-symmetric (respectively
symmetric) matrix.
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A natural question one could ask is whether the latter combinations are the only
possible ones from which to build skew-symmetric operators. It turns out they are not,
but that the missing operators can be written as linear combination of those appearing
in (92). To see this, let us consider a generic differential operator L=

∑
kLk(x, [ϕ])∂

k
x

that, for a given ϕ ∈ F, acts on perturbations δϕ ∈ TϕF, the Lk ’s being square matrices
that depend on x and ϕ. The skew-symmetric part LA of L reads

LA =
1

2

∑
k

[
Lk∂

k
x − (−1)k ∂kxL

>
k

]
, (93)

where L>
k is the transpose of Lk . Splitting each matrix Lk into its symmetric and skew-

symmetric parts, Lk = LSk +LAk , and rearranging the terms, we get

LA =
1

2

∑
k

{[
LAk ∂

k
x +(−1)k ∂kxL

A
k

]
+
[
LSk∂

k
x − (−1)k ∂kxL

S
k

]}
. (94)

Distinguishing derivatives of even and odd degrees, we finally obtain

LA =
1

2

∑
ℓ

{[
LAk ∂

2ℓ
x + ∂2ℓx LAk

]
+
[
LSk∂

2ℓ
x − ∂2ℓx LSk

]
+
[
LAk ∂

2ℓ+1
x − ∂2ℓ+1

x LAk
]
+
[
LSk∂

2ℓ+1
x + ∂2ℓ+1

x LSk
]}

. (95)

We thus see that any skew-symmetric differential operator can be written as the super-
position of 4 types of elementary skew-symmetric operators:

A∂2ℓx + ∂2ℓx A , (96)

S∂2ℓx − ∂2ℓx S , (97)

A∂2ℓ+1
x − ∂2ℓ+1

x A , (98)

S∂2ℓ+1
x + ∂2ℓ+1

x S , (99)

where A and S are matrix-valued function(al)s of x and ϕ that are antisymmetric and

symmetric, respectively. Let us denote by Â, S̄,Ā, and Ŝ the vector spaces respectively
generated by linear combinations of antisymmetric operators of the types (96)–(99). For

instance, the elements of Â are of the form
∑

ℓAℓ∂
2ℓ
x + ∂2ℓx Aℓ, where the sum is finite

and all the Aℓ are antisymmetric matrices that depend on x and ϕ.
Note that the operators that make up the generic cycle affinity operator (92) belong

either to Â or Ŝ. As the matrices α(ℓ),β(ℓ) in the expression (80) of γ can be chosen
arbitrarily in the spaces of antisymmetric and symmetric matrices, respectively, we

conclude that, as suggested by the notations, Â and Ŝ are the images under hat of A
and S ≡ Sself ⊕Sinter, respectively.
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We show in appendix F the following decomposition formulas for operators of the
form (97) and (98):

S∂2ℓx − ∂2ℓx S=−
ℓ−1∑
k=0

b2ℓ2k+1

[(
∂2ℓ−2k−1
x S

)
∂2k+1
x + ∂2k+1

x

(
∂2ℓ−2k−1
x S

)]
, (100)

and

A∂2ℓ+1
x − ∂2ℓ+1

x A=−
ℓ∑

k=0

c2ℓ+1
2k

[(
∂2ℓ+1−2k
x A

)
∂2kx + ∂2kx

(
∂2ℓ+1−2k
x A

)]
, (101)

with the same coefficients bℓk and cℓk as in equations (76) and (77). We thus see that
the operators of the form (97)(respectively (98)) can be written as a superposition of
operators of the form (99) (respectively (96)). In other words, we have the inclusions

S̄ ⊂ Ŝ and Ā ⊂ Â and it follows that the vector space of antisymmetric differential

operators (93), that we denote by LA, can be decomposed as LA = Â+ Ŝ. In particular,
this implies that the map hat is surjective from Ω2

loc to LA, i.e. that any element in
LA is of the form γ̂, with γ ∈ Ω2

loc. But an element γ̂ ∈ LA vanishes iff, for all δϕ1,δϕ2,´
δϕ1 · γ̂(δϕ2)dx= 0, which also reads γ(δϕ1,δϕ2) = 0, by definition of hat. Using (79)

we conclude that

γ̂ = 0⇔α(ℓ) = β(ℓ) = 0 . (102)

and ker(hat) = {0}. Consequently we have the direct-sum decomposition of LA:

LA = Â⊕ Ŝ , (103)

and hat is a linear isomorphism between Ω2
loc and LA.

To make the correspondence between decomposition (103) and its counterpart for
two-forms even clearer, let us consider a generic γ ∈ Ω2

loc(F), but start from its expres-
sion (72) rather than its decomposition (80) in the basis (78). On the one hand, we can
decompose each matrix γ(k) = Sγ(k)+ Aγ(k) into its symmetric and antisymmetric parts,
as in section 4.1. Then, we notice that formulas (73) and (74) mean that the components

of γ of the form Aγ
(2ℓ+1)
x : δx ∧ ∂2ℓ+1δx and Sγ

(2ℓ)
x : δx ∧ ∂2ℓδx can be respectively decom-

posed along the elementary two-forms (δx ∧ ∂2kδx)k⩽ℓ and (δx ∧ ∂2k+1δx)k⩽ℓ, leading to
the expression (80), with coordinates (76) and (77). On the other-hand, applying the
hat map to the expression (72) of γ gives an alternative formula for γ̂:

γ̂ =
∑
k

{
(−1)kγ(k)∂k− ∂k

[
γ(k)

]>}
, (104)

which coincides with the generic expression of a skew-symmetric differential oper-
ator (93), with Lk = 2(−1)kγ(k). Repeating for γ̂ the reasoning we had above for the
operator LA, we end up decomposing the operators [Sγ(2ℓ)]∂2ℓ− ∂2ℓ[Sγ(2ℓ)] ∈ S̄ and
[Aγ(2ℓ+1)]∂2ℓ+1− ∂2ℓ+1[Aγ(2ℓ+1)] ∈ Ā respectively using formulas (100) and (101), which
gives back the expression (92) of γ̂. Hence, the decomposition formulas (100) and (101)
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in LA (and the corresponding direct sum decomposition (103)) mirror formulas (73)
and (74) in Ω2

loc(F) (and its corresponding decomposition), this exact correspondence
being given by the isomorphism hat.

As an example of this correspondence, let us consider the cycle affinity operator ω̂
of AMB in d1=1 dimension. Using definition (39) together with expression (67) of ω
yields, after some integrations by parts,

ω̂ρδρ= {∂x [(2λ∂xρ)δρ] + 2λ(∂xρ)δρ}+
{
−κ∂2xδρ+ ∂2x (κδρ)

}
. (105)

Let us denote by ω̂(1) and ω̂(2) the two operators within each pair of curly brackets on

the right-hand side of equation (105). We see that ω̂(1) ∈ Ŝ while ω̂(2) ∈ S̄. Consequently,
these operators are not independent26 and the latter can be re-written as

ω̂(2)
ρ δρ≡−κ∂2xδρ+ ∂2x (κδρ) = δρ∂2xκ+2(∂xκ)(∂xδρ) = ∂x [(∂xκ)δρ] + (∂xκ)(∂xδρ) ,

(106)

so that the whole cycle affinity operator also reads

ω̂ρδρ= ∂x [(2λ+κ ′)(∂xρ)δρ] + (2λ+κ ′)(∂xρ)∂xδρ . (107)

This mirrors, at the level of the skew-symmetric operator ω̂, what happens for the
vorticity 2-form ω, where the second term on the right-hand side of the expression (67)
can be decomposed along the same elementary two-form as the first one. Comparing
the form (107) to the generic expression (92), ω̂ has a single non-zero component:

β
(0)
11 =−(2λ+κ ′)∂xρ, along the elementary operator of order ℓ= 0 of the self-symmetric

family. The fact that the latter is ‘free’ (in the sense of (102)) provides an alternative
way to find the reversibility condition of AMB: 2λ+κ ′ = 0.

Hence, the results of this section allow the irreversiblity of dynamics (8) – in d1=1
spatial dimension and with a one-form D−1a that is local—to be seen from the point
of view of the cycle affinity operator ω̂. We see that, from the four different types
of differential operators (96)–(99), two are redundant, while the other two are ‘free’
in an appropriate sense (102) which allows us, in particular, to directly deduce the
explicit reversibility condition(s) of the dynamics. These properties of antisymmetric
differential operators mirror (and hopefully illuminate) the corresponding ones found
earlier for local two-forms.

4.4. Phenomenology of each vorticity subspace

In this section, we examine what phenomenology one could expect from a dynamics (8)
whose vorticity two-form ω belongs exclusively to one of the three subfamilies of (78)
identified in 4.1. Of course, determining the precise phenomenology of a field theory
only based on the corresponding ω is not completely possible, as the latter only con-
tains linearized information about what makes the dynamics irreversible. However, we
will see that tackling this problem through the vorticity dynamics (47) – even with

26 By ‘independent’, we here mean that ω̂ = 0 is not equivalent to ω̂(1) = ω̂(2) = 0, since Ŝ ∩ S̄ = S̄ 6= 0.
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rather generic forms of this operator—allows us to qualitatively recover celebrated, typ-
ically out-of-equilibrium, behaviors, from the flocking state of aligning self-propelled
agents to the run-and-chase dynamics of non-reciprocally interacting mixtures, through
nonequilibrium pattern formation.

Once again, we here focus our attention only on d1=1 dimensional dynamics obey-
ing (8) whose one-form D−1a is local in ϕ so that the corresponding vorticity two-form
ω ≡ dD−1a can be expended on the basis (78). Even though generically the vorticity
has no reason to be generated by only one of the subfamilies identified in (78), we will
assume below that this is the case and examine each subspace successively. As our ana-
lysis is essentially qualitative, we expect the behavior of a superposition of vorticities
from distinct subfamilies of (78) to be in large part the superposition of the corres-
ponding phenomenologies. Note however that the methods used below to analyze each
subfamily independently could easily be adapted to a superposed case.

We start by rewriting here for convenience the dynamics (47) generated by the
vorticity operator:

∂tδϕ=Wϕδϕ , (108)

which encapsulates the time-irreversible part of dynamics (8) in the vicinity of a given
ϕ. Let us recall that, as stated in section 3.2, the vorticity and cycle affinity operators
are related by W=−Dω̂/2.

For simplicity, we assume from now on the diffusion operator D to be proportional
to the identity, unless otherwise stated explicitly. We can further assume this (positive)
constant be equal to one, as any other one could be subsumed in the coordinates of
the generic vorticities we will consider. We will briefly comment below how our results
generalize to other situations. In particular, having D∝ ∂2x (which is often the case for
conserved fields) does not change the qualitative results found below.

For concreteness, as well as setting d1=1 we focus on the case d2=2 in this section.
(Recall that d2 is the dimension of the order parameter space.) Nonetheless we will
argue below—notably through the example of non-reciprocal flocking in section 4.4.1—
that, in higher d2 dimensions, the typical phenomenology associated to each subspace
of (78) remains very similar in Rd2>2 as compared to R2. However when ϕ is not a ‘true’
Rd2-valued vector field but rather a collection of various fields (of e.g. number density
and polarity; see the example of Active Ising Model (ATM) at the end of this section)
stacked together, the way this phenomenology is observed in the ‘physical space’ Rd1

may appear quite different.

4.4.1. The antisymmetric subspace and non-reciprocal interactions. Let us consider a
cycle affinity operator that belongs to the antisymmetric subspace and is of homogen-
eous degree: ω̂ =α∂2ℓx + ∂2ℓx α, with α an antisymmetric matrix that depends on27 the
space variable x. Since D is assumed to be the identity, the vorticity operator reads

W=−1

2

[
α∂2ℓx + ∂2ℓx α

]
. (109)

27 Throughout section 4.4, we consider that ϕ is fixed and we study the linear dynamics (108) around this point in function space.
That is why we consider α as a function of x only.

https://doi.org/10.1088/1742-5468/add0a2 37

https://doi.org/10.1088/1742-5468/add0a2


Geometric theory of (extended) time-reversal symmetries in stochastic processes: II. Field theory

J.S
tat.

M
ech.(2025)

053204

Let us first consider the case ℓ= 0 which is slightly degenerate. In this case, W acts
as a multiplication by the antisymmetric matrix −α, which generically depends on x.
The solution of (108) hence corresponds to a field δϕ that rotates on site at each x ∈ R –
i.e. all δϕ(x) independently rotate in R2—in a direction (clockwise or counter-clockwise)
and with a speed that are given by −α12(x) = α21(x).

Let us now turn to the case ℓ⩾ 1. We start by considering the first of the two limit-
regimes described in section (3.2), where the fluctuation δϕ initially varies on a spatial
scale ℓδϕ that is much larger than that for spatial variations of the operator W (which is
itself that of the matrix α and in turn depends on the chosen base-state ϕ), ℓδϕ � ℓW .
In such a regime, W again acts as multiplication by an antisymmetric matrix, which is
−∂2ℓx α/2 in this case. Consequently, the phenomenology is the same as that of the ℓ= 0
case, although the role previously played by α is now taken by ∂2ℓx α/2. Note that if α
is uniform, then ℓW =∞ and this first regime does not exist.

In the opposite limit-regime, where we consider fluctuations δϕ that vary on much
smaller scales than W, ℓδϕ � ℓW , we partition the physical space Rd1 = R into sub-
domains where α can be considered uniform and, consequently, where the vorticity
operator approximately reads W'−α∂2ℓx . In Fourier space, the latter thus acts as a
matrix multiplication by:

Wk =Wk

[
0 −1
1 0

]
, (110)

where Wk ≡ (−1)ℓα12k
2ℓ and k is the wave number. If we focus on a generic harmonic

mode that initially reads

δϕk (x, t= 0) =

[
ρ1 cos(kx+ θ1)
ρ2 cos(kx+ θ2)

]
, (111)

then the solution at time t is

δϕk (x, t) = etWk

[
ρ1 cos(kx+ θ1)
ρ2 cos(kx+ θ2)

]
=

[
ρ1 cos(kx+ θ1)
ρ2 cos(kx+ θ2)

]
cos(Wkt)+

[
−ρ2 cos(kx+ θ2)
ρ1 cos(kx+ θ1)

]
sin(Wkt) . (112)

Compared to the previous limit-regime, W can still be seen as a generator of rotations
but the rotation speed now increases with the wavenumber k. Moreover, the vector
δϕk(x, t) ∈ R2 always rotates at the same speed and in the same direction at all x in a
given domain within which α12 is considered uniform. Interestingly, the solution (112)
can also be written as the superposition of propagating waves (see appendix G.1):

δϕk (x, t) = ρ+

[
cos(kx+Wkt+ θ+)
sin(kx+Wkt+ θ+)

]
+ ρ−

[
cos(kx−Wkt− θ−)
−sin(kx−Wkt− θ−)

]
. (113)
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In equation (113), ρ± and θ± are the polar coordinates of the vectors (U ±V )/2 ∈ R2,
i.e.

U ±V

2
= ρ±

[
cosθ±
sinθ±

]
, (114)

where

U ≡
[
ρ1 cos(θ1)
ρ2 cos(θ2)

]
and V ≡

[
−ρ2 sin(θ2)
ρ1 sin(θ1)

]
. (115)

We see in equation (113) that the ‘+ ′ (respectively ‘− ′) component of δϕk (which
are respectively defined as the first and second term on the right-hand side of
equation (113)), which is positively (respectively negatively) circularly polarized,
propagates on R at speed Wk/k = (−1)ℓα12k

2ℓ−1 in the direction given by sign(−Wk)
(respectively sign(Wk)). To further interpret these facts, let us assume that, for instance,
Wk > 0. Then we see that in both the ‘+ ′ and ‘− ′ component in (113), δϕ2k has a phase
delay of π/2 with respect to δϕ1k in the direction of propagation. In other words, if we
interpret the components δϕ1,2 as representing two different ‘species’, then everything
happens as if δϕ2k was chasing δϕ1k (see figure 2).

Interestingly, if α12 changes its sign over R, a given component chases the other on
all sub-domains of a given sign of α12, while the contrary happens on the sub-domains
of opposite sign. Besides, if α12 has a constant sign over all R, but if the sign of ∂2ℓx α12 is
different from that of α12, then the attribution of the pray and predator roles depends
not on the spatial region but on the spatial scale.

A lot of attention has been recently devoted to non-reciprocally interactive mixtures,
notably for their relevance in biology. When the interacting fields are scalar, the non-
reciprocity of their interactions has been identified as a generic route to oscillating and
traveling patterns, from the non-reciprocal Swift–Hohenberg (NRSH) model [38] to the
non-reciprocal Cahn–Hilliard (NRCH) system [39–42]. In the NRCH, the operator b
is made up of several divergence operators stacked on top of each other (one for each
species), i.e. b= (∇·, . . . ,∇·)>, while in the Swift-Hohenberg model28 b is usually taken
to be the identity (we disregard any multiplicative constant here). In the various versions
of the NRSH and NRCHmodels cited above, the drift is always of the form a=Dζ where
ζ =−δF/δϕ−αϕ, α being a spatially-uniform matrix that is not symmetric and hence
breaks the reciprocity of the interactions. (We here consider that α is antisymmetric,
as its symmetric part can always be absorbed in the functional derivative term in ζ.)
In both cases, ω = dζ = αijδ

i ∧ δj and ω̂ = 2α so that they belong to the antisymmetric
subspace and are of order ℓ= 0. Their respective vorticity operator also belongs to
the antisymmetric subspace, with that of the NRSH being of order ℓ= 0 while that
of the NRCH is of order ℓ= 1. Indeed, while the diffusion operator is the identity in
the former model, so that W=−ω̂/2 =−α, it is the identity matrix multiplied by
minus the Laplacian operator in the latter, so that W=∆ω̂/2 =α∆. Note that, as

28 The non-reciprocal Swift–Hohenberg model that appears in [38] is purely deterministic. However, no field is conserved in this
model so the dominant noise term at large scales should be proportional to the identity operator, a case often considered in the
literature on the classical (i.e. reciprocal) Swift–Hohenberg model [43–46].
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Figure 2. A schematic picture of the (short-scale) phenomenology we expect from
each subspace of the decomposition Ω2

loc(F) =A⊕Sself ⊕Sinter. The dark- and light-
green curves represent the components δϕ1 and δϕ2, respectively, while the arrows
give their direction of propagation. The left (respectively right) panel illustrates
the behavior of δϕ1,2 when ω belongs to the antisymmetric subspace A (inter-
symmetric subspace Sinter, respectively) for given order ℓ and coefficient α12 (resp.
β12): the components propagate in a common direction which depends on whether
their phase difference ∆θ belongs to (−π,0) or (0,π) (respectively to (−π/2,π/2)
or (π/2,3π/2)). The top panel illustrates the behavior of a component δϕi when ω
belongs to the self-symmetric subspace Sself : it propagates in a direction that solely
depends on the order ℓ and the coefficient βii .

announced in the beginning of section 4.4, the fact that D∝∆ in the NRCH model
only changes the order of the derivative and not the subspace to which W belongs, as
compared to ω or ω̂. All the references cited above about these two models have reported
oscillatory and propagative behaviors as if one component was chasing the other, which
is in accordance with the classification proposed in section 4 and its corresponding
phenomenological picture. This is, surprisingly, in spite of their respective stationary
probability not being concentrated in the vicinity of a given static profile as it is the case
e.g. for the AMB. Finally, it is worth emphasizing that the matrix α in these models
is always considered uniform, so that the possible exotic dependence on the spatial
subdomain or spatial scale of which component is ‘chasing’ the other (as mentioned at
the end of the previous paragraph) should not appear and does not seem to have been
observed. It would thus be most interesting to either find or invent such a model.

Another example of a dynamics whose vorticity two-form belongs to the antisym-
metric subspace A is given the following reaction-diffusion dynamics between species u
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and v

∂tu=∆u+P (u,v)+
√
Duηu , (116)

∂tv =∆v+Q(u,v)+
√
Dvηv , (117)

where the strictly-local functionals P and Q are the reaction terms, Du and Dv are
constants, η(x, t)≡ (ηu,ηv)

> is a random field with the same statistical properties as in
equation (8), and the space-time units are chosen such that the diffusion constants of
u and v are set to unity. Note that the noise should also contain conservative terms
arising from diffusion, but these are typically negligible when compared to non-conserved
terms on sufficiently large spatial scales. The vorticity two-form associated with dynam-
ics (116) and (117) is straightforwardly shown to read

ω =

(
D−1
u

∂Px
∂v

−D−1
v

∂Qx

∂u

)
δvx ∧ δux , (118)

and hence indeed belongs to the antisymmetric subspace A, in accordance with
the traveling patterns notoriously observed in out-of-equilibrium reaction-diffusion
equations [47].

When the field ϕ takes values in an Euclidean space of dimension d2 > 2, the gen-
eric phenomenological picture of the antisymmetric subspace depicted above for d2=2
remains very similar when observed in Rd2, although its physical manifestation may
appear different at first sight. Indeed, for any antisymmetric matrix α of size d2× d2,
there exists a basis in which α can be block-diagonalized, with each block being two-
by-two and of the form of the right-hand side of equation (110) (in odd dimension,
there is an additional column of zeros in the matrix) [48]. The phenomenology of the
dynamics of each projection of δϕ onto one of the two-dimensional subspaces of Rd2 cor-
responding to a block is hence the same as the generic two-dimensional phenomenology
depicted above. The global phenomenology is then a superposition of that of each two-
dimensional projection. This similarity might be hard to perceive when ϕ represents
e.g. a pair of two-dimensional vector-field stacked together, in which case one directly
observes the collective time-evolution of the two vector fields over R2 rather than that
of ϕ in R4. This is the case for instance in the field dynamics presented in [38] which is
the coarse-grained hydrodynamics of a mixture of two species of self-propelled particles
where one species tries to align with the second, while the latter tries to anti-align with
the former. The authors of this article reported several non-equilibrium phases, namely
a chiral phase, a swap phase, and phase that is both chiral and swap. In appendix H, we
study a stochastic version of this model and show its vorticity two-form to belong to the
antisymmetric subspace. We then show that the coordinates of this vorticity two-form
accounts for the chiral, swap, and chiral-swap phases (at least at linear order).
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4.4.2. The symmetric subspace: phase separation, interface growth, and flocking.
We now consider a cycle affinity operator of the symmetric subspace that reads
ω̂ =−(β∂2ℓ+1

x + ∂2ℓ+1
x β) where ℓ is an integer and β an x -dependent symmetric matrix.

Again, since D is assumed to be the identity, the associated vorticity operator is

W=
1

2

[
β∂2ℓ+1

x + ∂2ℓ+1
x β

]
. (119)

Below, we separate the analysis of self-symmetric and inter-symmetric terms in the
matrix β. This may seem redundant at first sight since β, as a real symmetric matrix,
can always be diagonalized in an appropriate basis in which, in turn, ω would belong
to the self-symmetric subspace. And indeed, if the field ϕ is a proper Rd2-valued vector
field, then changing the basis amounts to adopting an equivalent representation, and the
study boils down to the case where β is diagonal. However, if ϕ is not a true vector field,
but rather a collection of different fields (e.g. of mass and polarity) stacked together,
then changing basis in Rd2 may mix components of different natures and hence does
not make sense from a physical standpoint. In the latter case, (block-) diagonal and off-
(block-)diagonal terms in β are drastically different, as they respectively correspond to
self- and cross-interactions of the various fields that composed ϕ. We still focus on the
d2=2 case and further assume that the two components of ϕ represent different (scalar)
fields. Consequently, β is a two-by-two matrix whose self-symmetric (respectively inter-
symmetric) components correspond to the diagonal (respectively off-diagonal) ones.

4.4.2.1. Self-symmetric subspace. In this paragraph, we consider the case where β is
diagonal, i.e. β12 = β21 = 0. Just as we previously did for the antisymmetric subspace,
we start by considering the limit-regime where ℓδϕ � ℓW in which the vorticity operator
acts by multiplication by the symmetric matrix ∂2ℓ+1

x β/2:

W'
[
∂2ℓ+1
x β/2

]
=

[
∂2ℓ+1
x β11/2 0

0 ∂2ℓ+1
x β22/2

]
. (120)

If [∂2ℓ+1
x β/2] 6= 0—which exclude in particular the case where β is independent of

x—then the i th component of ϕ either increases or decreases exponentially at rate
∂2ℓ+1
x βii/2, which typically happens until ℓδϕ ∼ ℓW , a time at which the approxima-

tion (120) is no longer valid. Note that, as this regime must hence be transient, its
nature is quite different from that of the same limit in the antisymmetric subspace. It
does not describe the irreversible evolution of fluctuations in the vicinity a given profile,
but rather a shift in the latter profile, as we saw for the AMB example in section 3.2.

In the opposite limit-regime, when ℓδϕ � ℓW , the vorticity operator approximately
reads

W' β∂2ℓ+1
x =

[
β11 0
0 β22

]
∂2ℓ+1
x . (121)

Then, if we focus on a generic harmonic mode perturbation δϕk that is initially of the
form (111), the solution of dynamics (108) is given by (see appendix (G.2))
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δϕk (t) =

[
ρ1 cos

(
kx+W 1

k t+ θ1
)

ρ2 cos
(
kx+W 2

k t+ θ2
)] , (122)

with

W j
k = (−1)ℓk2ℓ+1βjj . (123)

Hence, each component propagates independently along R at speed and direction
imposed by W j

k/k = (−1)ℓk2ℓβjj . In [14], the author showed the AMB and the KPZ
equation to display such a phenomenology, and proved that their vorticity two-forms
are both generated by the self-symmetric subfamily of the basis (78). Note that this
fact is directly implied by two properties shared by the AMB and the KPZ dynam-
ics: their respective one-forms D−1a are both local in the field; moreover both these
dynamics describes the time evolution of a sole scalar-valued field, i.e. d2=1, a case in
which the basis (78) reduces to the self-symmetric family. This confirms the intuition
that run-and-chase behavior cannot emerge from a single species model. Finally, the
phenomenological predictions made in [14] were based on a qualitative analysis of the
respective (functional) probability currents of AMB and KPZ. It is worth emphasizing
that these predictions can be obtained more straightforwardly and specified by com-
puting the corresponding vorticity operators W and analyzing their flow, as we have
demonstrated in section 3.2.2 for AMB. A similar analysis can be carried out for KPZ
dynamics, which reads:

∂th= κ∆h+λ|∇h|2+Dη , (124)

where h(x, t) is the height field, D the diffusivity constant, η a random field with the
same statistics as in equation (8), and κ(h(x, t)) and λ(h(x, t)) are considered as local
functions of h for greater generality. The vorticity two-form of KPZ equation coincides
with that of AMB (equation (37)), while its vorticity operator is readily found—using
formula (46) – to be:

W=−D
2
{(2λ+κ ′)∇h ·∇δh+∇· [δh(2λ+κ ′)∇h]} . (125)

4.4.2.2. Inter-symmetric subspace. Let us now turn to the inter-symmetric subspace,
which can be embodied by a matrix β whose diagonal coefficients are both identically
zero. In the first limit regime, where ℓδϕ � ℓW , W acts as a multiplication by the matrix
[∂2ℓ+1
x β/2]:

W' [∂2ℓ+1
x β/2] =

(
∂2ℓ+1
x β12/2]

)[0 1
1 0

]
. (126)

The solution of the vortex dynamics (108) is then

δϕ(r, t) =

[
cosh(νt) sinh(νt)
sinh(νt) cosh(νt)

]
δϕ(r,0) , (127)
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with ν ≡ ∂2ℓ+1
x β12/2. At time t� ν−1, this solution asymptotically becomes

δϕ(t)' e|ν|t

2

(
δϕ1 (0)+ sign(ν)δϕ2 (0)

)[ 1
sign(ν)

]
, (128)

i.e. at long time, if ν > 0 (respectively ν < 0), δϕ1 and δϕ2 becomes equal (respectively
opposite) and diverge exponentially fast at rate |ν(x)|, until ℓδϕ ∼ ℓW , at which point
approximation (126) is not longer valid. Just as in the self-symmetric case, this regime
should not be seen as a heuristic description of the fluctuations’ dynamics in steady
state around a typical profile, but rather a contribution to the creation of this typical
profile.

In the opposite ℓδϕ � δW regime, the vorticity operator (119) is approximately given
by

W' β∂2ℓ+1
x = β12

[
0 1
1 0

]
∂2ℓ+1
x . (129)

The solution of dynamics (108) starting from a pure harmonic perturbation δϕk(0)
given by equation (111) reads:

δϕk (x, t) = ρ+ cos
(
kx+W 1

k t+ θ+
)[1

1

]
+ ρ− cos

(
kx−W 1

k t+ θ−
)[ 1

−1

]
, (130)

where W 1
k = (−1)ℓk2ℓ+1β

(ℓ)
12 , and ρ

±,θ± are given in appendix G.2. We see that, in this
case, the ‘+’ and ‘−’ components, which are respectively defined as the first and second
term of the right-hand side of equation (130), have coordinates δϕ1k,δϕ

2
k that are respect-

ively in phase and phase opposition and propagate on R in the directions sign(−Wk)
and sign(Wk), respectively (see figure 2).

In figure 2, we summarize the typical behavior of both the antisymmetric and inter-
symmetric subspaces in the ℓδϕ � ℓW regime. Their main difference is that the direction
of propagation depends on whether ∆θ belongs to (−π,0) or to (0,π) in the antisymmet-
ric subspace, while it depends on whether ∆θ belongs to (−π/2,π/2) or to (π/2,3π/2)
in the inter-symmetric subspace, where ∆θ denotes the phase difference between δϕ1

and δϕ2. In other words it depends on which component is ‘behind the other’ in the
former case, and on whether these components are ‘together or apart’ in the latter.

Interestingly, to the best of our knowledge, there is no field theory in the literature
describing the collective dynamics of the densities of two active species whose vorticity
two-form belongs to the inter-symmetric subspace. In such a case, it could describe a
kind of cooperation phenomenon between the two species: if they are co-localized, they
propagate in one direction, while if they are demixed, they propagate in the other.

On the other hand, if we now think about the components of δϕ as being respectively
a density and a polarization in one spatial dimension, then the inter-symmetric phe-
nomenology depicted above strikingly resembles that of flocks of aligning self-propelled
particles. To confirm this correspondence, we now consider a stochastic (coarse-grained)
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AIM [49], which reads:

∂tρ=D∂2xρ− v∂xm+ ∂x
√
2Dηρ , (131)

∂tm=D∂2xm− v∂xρ+ γ1m+ γ2m
3+

√
2Dηm , (132)

where D is a diffusion constant, v is the self-propulsion speed, and γ1,2 parametrize
the aligning interactions. In the original version of the AIM, γ1 is constant whereas γ2
depends on ρ(x). This latter fact would generate a term in the vorticity two-form that
stems from an irreversibility in the alignment interaction (see appendix I). As we want
to focus here on the irreversibility that results from the self-propulsion only, we consider
a simplified version of the model where γ2 is also constant. In equations (131) and (132),
ηρ,m(r, t) are independent random Gaussian fields whose statistics are the same as the
components of η in equation (8). These noise terms are absent in the hydrodynamic
equation initially derived from the microscopic AIM [49]. We add them here to account
for the macroscopic fluctuations around the hydrodynamic limit in the simplest possible
way29 that is compatible with the fact that ρ is conserved and m is not. Consequently,
the resulting dynamics (131) and (132) can be seen as a stochastic diffusion equation
and a model A dynamics that are coupled together by self-propulsion.

In appendix I, we show the vorticity two-form of dynamics (131) and (132) to read

ω ≡ dD−1a=− v

D
δρx ∧ ∂δmx+ v

D
Gxyδ

ρx ∧ ∂δmy , (133)

where Gxy ≡G(x− y) is the Green function of the Laplacian in one dimension, i.e.
∂2xG(x− y) = δ(x− y). As anticipated, ω has a component along the inter-symmetric
subfamily: the first one on the right-hand side of equation (133). Interestingly, ω
also possesses a non-local component, the second term on the right-hand side of
equation (133), and is thus not entirely generated by the local vorticity basis (78).
Note that this does not contradict our general result about the fact that the family (78)
is a basis for the space Ω2

loc(F) precisely because the one-form D−1a of dynamics (131)
and (132) is non-local. Despite the presence of this non-local component, we show in
appendix I that the vorticity dynamics (47) associated to the two-form (133) displays a
phenomenology very similar to that of the inter-symmetric subfamily, described above
and summarized in figure 2. More precisely, a harmonic perturbation whose density and
polarity components are in phase propagates in the direction of increasing x, while it
propagates in the opposite direction when the components are in antiphase. This con-
firms the heuristic correspondence drawn above between the phenomenology one could
expect from the inter-symmetric subspace and collective motion.

In the next subsection, we discuss the results of subsections 4.1–4.4 and their limit-
ations, and elaborate on their possible extensions to broader situations.

29 Note that the structure of the coasre-grained noise was explicitly computed in [50] for several versions of AIM, not including our
constant γ2 AIM.
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4.5. Discussion

In section 4, we have constructed a basis of the space Ω2
loc(F) of local two-forms in d1=1

dimension. This basis first provides explicit reversibility condition(s) for a dynamics (8)
whose one-form D−1a is local in ϕ. Using the vortex dynamics (47), we then showed
that it could be decomposed in three subfamilies, with the elements of each displaying
generic phenomenologies. Surprisingly, this approach exposes many celebrated out-of-
equilibrium phenomena of which it provides a unified description. This viewpoint could
also be useful to ‘transport a phenomenology’ from an active field theory to another,
as we have seen that e.g. the flocking behavior of the symmetric family has not been
observed yet in mixture of active species, where it could be interpreted as describing
some sort of cooperative behavior.

However, we point out that the correspondence between the subspace of Ω2
loc(F)

and the out-of-equilibrium phenomenology described above strictly applies only when
the diffusion operator D is proportional to the identity, since the typical irreversible
phenomenology of an out-of-equilibrium dynamics of the form (8) is given by the
vorticity operator W=−Dω̂/2 rather than by the cycle-affinity operator (or equival-
ently the vorticity two-form ω). Interestingly, this correspondence remains qualitatively
unchanged on small scales ℓδϕ � ℓW when

D '
ℓδϕ�ℓW

∑
p

Dp∂
2p
x (134)

where each Dp is a constant scalar. This is because an element of ω̂, belonging to one of
the three identified subspaces, remains in that subspace upon multiplication by a deriv-
ative of order two. But a field theory whose diffusion operator is not of the form (134)
on small scales could display an irreversible phenomenology which deviates from those
predicted above for the same vorticity two-form. For such a diffusion operator, the gen-
eral phenomenological study we conducted in 4.4 should thus be adapted to describe
the class of stochastic dynamics (8) sharing this given D.

Besides, in spatial dimension d1 > 1, the phenomenology of the family (88) is very
similar to its one-dimensional counterpart (78). Nevertheless, we have seen in section 4.2
that, contrary to the d1=1 case, the family (88) is not a basis of the space of local
two-forms Ω2

loc(F). Thus, this family remains to be completed appropriately, and the
phenomenology of the resulting additional subspace C of Ω2

loc(F) explored, in future
work.

We have also seen, with the example of the AIM, that the one-form D−1a of dynam-
ics (8) can be non-local in ϕ, in which case a basis of local vorticities is not sufficient
to decompose the corresponding vorticity ω ≡ dD−1a. We denote by Ω2(F) the space
of arbitrary two-forms (i.e. which are not necessary local) and N its subspace which is
made of purely non-local two-forms30. The question of whether any general properties
of the elements of N could be exhibited remains to be studied.

30 In general ω = ωijxyδix ∧ δjy . We say that a two-form ω is purely non local iff ωijxy does not contain Dirac δ(x− y) nor any of
its derivatives in any direction.
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Importantly, we proved the family (78) to be a basis of two-forms only when the space
M on which the field ϕ is defined is the real line,M = R. This proof can easily be adapted
if M is the circle but, if there are boundaries, it fails and the family (78) must then be
completed with two-forms that are localized at the boundary ∂M of M 31. Similarly, if
the dimension d1 of the space M is higher than one, the generalized decomposition (90)
is valid only when ∂M = ∅. When that is not the case, this decomposition should be
completed with the space of vorticity two-forms that are localized atM, which we denote
by B. Although these vorticities ω ∈ B are beyond the scope of this article, it is worth
noting that they might be good candidates to systematically account for the notoriously
diverse and surprising behavior of active systems at their boundaries [51–53].

All in all, the space of two-forms Ω2(F), to which the vorticity of all dynamics of the
form (8) belongs, can be decomposed as

Ω2 (F) =A⊕Sself ⊕Sinter⊕C ⊕N ⊕B . (135)

Interestingly, we show in section 5 the entropy production rate of dynamics (8) to be
a linear functional of the vorticity ω. Consequently, (135) can be seen as a decompos-
ition of independent sources of entropy production. In section 4, we studied the first
three components of this decomposition, while the exploration of the others remains an
exciting challenge for the future.

Beyond the perspective of bringing order to the vast zoo of out-of-equilibrium field
theories, decomposition (135) could also be used to build a nonequilibrium dynamics
with desired properties. To this end, one could start from an equilibrium limit of the
dynamics that is sought, then construct a vorticity two-form with the appropriate com-
ponents in each subspace (135), then integrate it32 and multiply the resulting D−1a
by D to obtain a functional vector field whose addition to the equilibrium drift should
produce the desired effects, at least qualitatively. Finally, we will see in section 6 that
new sources of entropy production can add up to ω, either when considering a more
general notion of time-reversal, or when the space F is not simply connected.

5. Vorticity and entropy production: what is captured and what is missed

5.1. Entropy production and the vorticity 2-form

To further stress the role or the vorticity two-form ω in the possible TRS-breaking of
dynamics (8), we study in this section its relation to entropy production. In particular,
we show that ω can be interpreted as the entropy production per unit area in the space
F.

5.1.1. Path-wise entropy production. As stated at the beginning of section 3.1, all
the components of ϕ are supposed to be even under time-reversal (see section 6 for

31 By ‘localized at the boundary of M ’, we mean that these additional two-forms, applied to a pair (δϕ1,δϕ2) of fluctuations around
a given ϕ, only depend on the values of ϕ,δϕ1,δϕ2 and their derivatives (up to a finite order) at the boundary of M.
32 Note that to be integrated, the constructed two-forms must be exact. To verify that this is the case, one could try to use the
coordinates expression (81) and (82) of a generic exact two-form. But a more practical criterion would be to check whether the
exterior derivative of this two-form vanishes.
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a more general situation, involving odd degrees of freedom). In such a situation, the
path-wise entropy production [7]—more precisely the path-wise informatic entropy pro-
duction [54]—of dynamics (8) along a trajectory (ϕt)t∈T is defined as:

Σ̂
[
(ϕt)t∈T

]
≡ ln

P
[
(ϕt)t∈T

]
P
[(
ϕT −t

)
t∈T

] . (136)

A direct computation33, using e.g. the Onsager Machlup functional, shows Σ̂ to obey

Σ̂
[
(ϕt)t∈T

]
=

ˆ T

0

[
D−1a

]
ir
∂tϕ

irdt− lnPss [ϕT ] + lnPss [ϕ0] , (137)

where the stochastic integral is defined in the Stratonovich sense. We directly read from

this equation that, just as in finite dimension, Σ̂ interestingly does not depend on the
time-parametrization of the oriented path C ≡ (ϕt)t∈T. This fact further underlines the
role of geometry in the study of the behavior of dynamics (8) with respect to time-
reversal.

Dynamics (8) is reversible iff Σ̂ vanishes for every continuous path in F. It turns
out that this proposition remains true if the set of continuous path is restricted to the
set of continuous loops (this can be seen e.g. by comparing equations (139) and (143)
below). Therefore, let us now consider an oriented path C ≡ (ϕt)t∈T that is a loop in F,
i.e. such that ϕ0 = ϕT . The boundary terms in the expression (137) of Σ̂ then vanish
and the entropy produced along C reads

Σ̂ [C] =
ˆ
C
D−1a . (138)

In equation (138), the right-hand side stands for the integral of the one-form D−1a
along C, which can be computed explicitly via any parmetrization (ϕt)t∈T of C, in which
case it takes the form of the integral on the right-hand side of equation (137). Having
assumed that F is simply connected, there exists an oriented surface S ⊂ F of which C is
the boundary, a property that we denote by C = ∂S. Thanks to our functional Stokes’
theorem (see section 3.1 and appendix B) we deduce that

Σ̂ [∂S] =
ˆ
∂S

D−1a=

ˆ
S
dD−1a=

ˆ
S
ω , (139)

which is a generalization to functional spaces of a result recently obtained in finite
dimension [9]. In order to interpret what this last equation says about the nature of ω,
we can let the surface S become infinitesimal around a given ϕ ∈ F, S → δSϕ, so that

the entropy produced along this oriented infinitesimal surface is Σ̂[δS] = ωϕ · δSϕ. In

33 We do not reproduce this now classical computation in this article. But thanks to our geometrical conventions of notation, it
can be directly and straightforwardly deduced from the same computation in finite dimension (see for instance our companion
paper [15]) by replacing the finite dimensional indices i,j, . . . by their continuous analogs ir,jr ′, . . . and using the generalized
Einstein convention introduced in this article.
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this last equation ωϕ · δSϕ is an informal notation for ωϕ(δϕ1,ϕ2) = ωirjr ′[ϕ]δϕir1 δϕ
jr ′

2 ,
where δϕ1,δϕ2 ∈ TϕF spans δSϕ. Therefore, ω ≡ dD−1a can be interpreted as the entropy
production per unit (oriented) area in F, as claimed at the beginning of this section.

5.1.2. Entropy production rate. Along the lines of this interpretation, we can even
show that the (global) informational entropy production rate (IEPR) , which is defined
as

σ ≡ lim
T →∞

1

T
Σ̂
[
(ϕt)t∈T

]
, (140)

is itself a linear functional of ω. Indeed, a computation that is similar to what is done
in finite dimension (see e.g. [15]), first leads to the following expression of the IEPR:

σ =
〈[
D−1a

]
ir
∂tϕ

ir
〉
=

ˆ
F

[
D−1a

]
ir
J irssDϕ , (141)

where 〈. . .〉 designates the average in steady state and Jss is the stationary probability
current associated to dynamics (8). Let us denote by div the functional divergence
operator (with respect to the Lebesgue measure Dϕ), which associates to a vector field
v[ϕ] over F the scalar-valued functional

div (v)≡ δvir

δϕir
. (142)

Since Jss is stationary, it is divergence-free: div(Jss) = 0. Formally extending Hodge-de
Rham theory [55] to this functional context, because F is simply-connected, we can
conclude that there exists a functional, antisymmetric, contravariant tensor of order

two, C, such that Jss =−div(C), i.e. J irss =− δCjr ′ir

δϕjr ′
. In turn, we can inject the latter

expression into formula (141) and, upon (functionally) integrating by parts and using
the antisymmetry of C, we get

σ =
1

2

ˆ
F
C ·ω Dϕ , (143)

where C ·ω ≡ Cjr ′irωjr ′ir. We see that the IEPR is indeed a linear functional of the vor-
ticity two-form ω. Once again, this generalizes to field theory a result recently obtained
for finite dimensional systems [9]. Note that, because there is no stationary probability
current when ω = 0, i.e. when dynamics (8) is reversible, we can conclude that the pres-
ence of a non-vanishing Jss is a consequence of the irreversibility, which is itself driven
by a non-zero ω. Since C is simply a ‘primitive’ of Jss, we can interpret ω as the source
of entropy production in (143), while C is only a consequence of it. Further, following
our interpretation of ω from equation (139), we can in turn informally interpret C[ϕ] in
equation (143) as a weight over all the infinitesimal loops that surrounds point ϕ ∈ F.

https://doi.org/10.1088/1742-5468/add0a2 49

https://doi.org/10.1088/1742-5468/add0a2


Geometric theory of (extended) time-reversal symmetries in stochastic processes: II. Field theory

J.S
tat.

M
ech.(2025)

053204

5.1.3. Loop-wise entropy production and phenomenology of AMB. In this section, we
show how the loop-wise entropy production formula (139) can be used as an alternative
way of describing the irreversible phenomenology of AMB, as was first uncovered in [14]
and revisited in section 3.2. To do this, let us denote by ρss the average stationary
profile of a phase-separated droplet of liquid surrounded by a gaseous phase. We can
then consider a certain oriented loop C around ρss ∈ F and compute the corresponding

entropy production Σ̂[C]. If the latter is positive, it means that the ‘activity’ of the
field dynamics (19) favors the time evolution of the field in the direction corresponding

to the orientation of C. Conversely, if Σ̂[C]< 0, it means that the activity favors the
opposite evolution. Since we are going to use formula (139), we directly start from a
parametrized surface S ∈ F such that C = ∂S. To simplify the computations, we choose
d1=1, i.e. ρss is a 1d profile, centered at x =0, and we focus on the left boundary of
the droplet, for which x ∈ R<0. Note that the cycle-affinity two-form of AMB (37) being
spatially additive (it is a spatial integral), if we consider the symmetric evolution on
the other side of the droplet, the resulting entropy product is simply doubled.

We consider a surface S ⊂ F that is parametrized by the map R : [0,1]× [0,2π/|w|]→
F such that

R (τ , t) : x ∈ R<0 7→ ρ(τ , t,x)≡ ρss (x)+ τA(x)cos(kx−wt) , (144)

where k,w ∈ R, with k ⩾ 0 and w 6=0, and A(x ) is a spatially-varying amplitude that
is for now arbitrary. The boundary of S ≡R([0,1]× [0,2π/|w|]) is then the loop ∂S =
R(1, [0,2π/|w|]) (see figure 3). This oriented loop corresponds to an almost harmonic
perturbation of ρss which propagates over one wavelength 2π/k (hence eventually closing
the loop) either leftward or rightward, depending on the sign of w.

We can then explicitly compute the entropy production along ∂S (see appendix J).
Assuming for simplicity that 2λ+κ ′ is a constant (a simplification already made in [14]),
we get

Σ̂ [∂S] = sign(w)(2λ+κ ′)πk

ˆ
R<0

A2∂xρssdx . (145)

We see that, as long as A(x ) does not vanish at the interface, since ∂xρss ⩾ 0 on the
left-hand side of the droplet, the entropy production is positive iff w and 2λ+κ ′ have
the same sign. This means that, for instance if 2λ+κ ′ > 0, the activity of dynamics (19)
favors a propagation of the perturbation ρ− ρss from the gas to the liquid, and vice versa
if 2λ+κ ′ < 0, as predicted in [14]. Another interesting point is, because ∂xρss vanishes
in the liquid and gas bulks, the activity only influences perturbations at the interface. In

particular, if A(x ) vanishes at the interface, then Σ̂ = 0, which means that the activity
does not favor any propagation. On the contrary, for instance if A is constant at the
interface but vanishes deep in the bulks, we get

Σ̂ [∂S] = sign(w)πA2k (2λ+κ ′)(ρL− ρG) . (146)
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Figure 3. A schematic representation of a functional loop. The grey box on the
left-hand side represents the functional space F. The dark disk in it stands for the
surface S and the multicolored loop for its boundary ∂S. The color encodes the
variable t ∈ [0,2π], with R(1, t) parameterizing ∂S, while the whole disk is para-
meterized by R(τ , t). On the right-hand side, the black curve is a schematic of
the left liquid-gas boundary of the average stationary profile ρss (the latter being
represented by the black dot at the center of the disk on the left-hand side). The
colored curves on top of it correspond to R(1, t) for |w|t= 0,2π/3,4π/3,2π, with
R(1,0) =R(1,2π/|w|). The black arrow above the graphs represents the propaga-
tion of the wave as t increases. Note that, as in figure 1, we pictorially represent
ρss by the graph of the function tanh(x).

5.2. Hidden current and hidden entropy production

Many fields of interest in hydrodynamics and continuum mechanics describe conserved
quantities, as e.g.mass, momentum or energy. When studying the stochastic dynamics of
such a field, there exists a notion of entropy production rate that is more discriminating
than (140). It consists in observing not only the field ϕ, but also its associated (real
space) current j, and comparing their forward and backward joint statistics. We denote
this resolved IEPR by σϕ,j, while the one defined in (140) is from now on denoted by
σϕ and called the bare IEPR. It follows from the properties of the Kullback-Leibler
divergence that we always have σϕ,j ⩾ σϕ. The difference between the two, that we call
the hidden entropy production rate, is generated by a divergence-free component of the
current that we call the hidden current. The choice of the names ‘hidden current’ and
‘hidden IEPR’ is motivated by the fact that they cannot be inferred from observations
solely of ϕ and its variations, i.e. they are hidden from the space F to which the field
ϕ belongs [56].

As can be directly deduced from a geometrical argument, these hidden current and
IEPR are also invisible from the vorticity two-form, hence displaying a possible blind
spot of the latter in the study of the TRS-status of dynamics (8). Indeed, the space of
current at a given ϕ can be seen as a resolved version of the tangent space TϕF that we
project down on the latter when taking the divergence, erasing the invisible current in
doing so. But ω being a two-form over F, it can only access tangential data and hence
will necessarily be blind to the hidden current and, consequently, to the hidden IEPR
as well.
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We start by presenting our general results in section 5.2.1 before illustrating them
on the example of a conserved scalar field in section 5.2.2. Finally, in section 5.2.3, we
discuss the relation between the resolved and microscopic IEPR.

5.2.1. General case. We expect the existence of the hidden current and IEPR to be
allowed whenever the operator bϕ of dynamics (8) has a non-trivial kernel. However,
we here restrict our analysis to the case where this operator can be decomposed as

bϕ =Bbϕ , (147)

where B and bϕ are linear operators, the latter being such that bϕb
†
ϕ is invertible and the

former—which is typically minus a divergence operator or several divergence operators
stacked one on top of the other—being independent of ϕ and having a non-empty kernel.
The operator b turns a Rd3-valued field over Rd1 into a Rd4-valued one over Rd1 and B a
Rd4-valued field into a Rd2-valued field, both also over Rd1. We denote by Jϕ the image
of bϕ.

As the drift aϕ of dynamics (8) belongs to the image of b (this is necessary for
D−1a to be well defined), for all ϕ ∈ F there exists kϕ, a Rd3-valued field over Rd1, such
that aϕ = bϕkϕ. We now define the deterministic current : Jϕ ≡ bϕkϕ ∈ Jϕ, as well as
the ϕ-dependent fields

si1r1 ≡ bi1r1i3r3

δ

δϕi2r2
bi2r2i3r3

, (148)

hi1r1λ ≡ bi1r1i3r3
bi2r2i3r3

δ

δϕi2r2
λ , (149)

where λ is the reference measure. It follows from these definitions that a=BJ, hλ =
Bhλ, and s(1/2) =Bs so that Stratonovitch prescription of dynamics (8) can be rewritten
as

∂tϕ
r =Br

r ′jr
′
[ϕ] (150)

jr [ϕ] = Jr [ϕ] + sr [ϕ] + hrλ [ϕ] + brr ′ [ϕ] ·ηr ′
, (151)

where j is the Stratonovitch random current. The resolved entropy production rate is
now defined as:

σϕ,j ≡ lim
T →∞

1

T
ln

P
[
(ϕt, jt)t∈T

]
P
[(
ϕT −t,−jT −t

)
t∈T

] . (152)

We then show this resolved IEPR, that takes into account the statistics of both the field
and the Stratonovitch current, to be given by (see appendix K.1):

σϕ,j =

〈ˆ
j
[
bb†
]−1

Jdr

〉
. (153)
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On the other hand, we already showed (see equation (141)) the bare IEPR to read

σϕ ≡ lim
T →∞

1

T
ln

P
[
(ϕt)t∈T

]
P
[(
ϕT −t

)
t∈T

] =〈ˆ ϕ̇[bb†]−1
a

〉
, (154)

where the integral runs over Rd1.
To connect the resolved and bare IEPRs, we now assume that the space of currents

(at a given ϕ) admits the following decomposition (see appendix K.2):

Jϕ = Im
(
bϕb

†
ϕB

†
)
⊕ ker(B) . (155)

It follows that the deterministic current splits as

Jϕ =−bϕb
†
ϕB

†µ+JH , (156)

where JH is the hidden current. Using equations (147) and (150) together with a=
BJ=−Bbb†B†µ the bare IEPR reads:

σϕ =−
〈ˆ

ϕ̇µ

〉
=

〈ˆ
j
[
bb†
]−1 [−bb†B†µ

]〉
. (157)

We can finally conclude that the resolved IEPR linearly splits as

σϕ,j = σϕ+σH , (158)

where the hidden entropy production rate σH is given by

σH ≡
〈ˆ

j
[
bb†
]−1

JH

〉
. (159)

Since the Kullback-Leibler divergence is non-decreasing upon marginalization, the hid-
den IEPR is always non-negative, σH ⩾ 0. In some situations, the hidden current JH and
the corresponding hidden IEPR σH can vanish, as is the case e.g. for the AMB dynam-
ics (19) and (20), so that σϕ, j = σϕ. Another possibility is that σϕ = 0 while σϕ,j 6= 0,
in which case dynamics (150) and (151) appears time-reversible from the statistical
properties of the sole field ϕ, while it is not as soon as the current j is also taken into
account [56].

5.2.2. The example of a conserved scalar field. To illustrate the notions of hidden
current and IEPR on a more concrete example, let us consider a conserved scalar field
ρ(r, t) whose dynamics is given by:

∂tρ(r, t) = −∇ · j(r, t) , (160)

j(r, t) = J(r, [ρt])+ s(r, [ρt])+M1/2 (r, [ρt]) ·η (r, t) , (161)
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where η is a noise with the same statics as in equation (7), and M a (positive definite)

mobility matrix. In the notations of section 5.2.1, B=−∇·, b=M1/2, and s is given
by equation (148). On the other hand, in the notations of equation (8), the drift is

a=−∇ ·J, the operator b=∇·M1/2, and the diffusion operator D≡ bb† reads D=
−∇ ·M∇. Finally, we choose the ‘functional Lebesgue measure’ as the gauge λ so that,
as detailed in section 2, hλ = hλ = 0.

The bare IEPR of dynamics (160) and (161) reads

σρ ≡ lim
T →∞

1

T
ln

P
[
(ρt)t∈[0,T ]

]
P
[
(ρT −t)t∈[0,T ]

] = 〈ρ̇r [D−1a
]
r

〉
=

〈ˆ
dr ρ̇ [∇·M∇]−1∇·J

〉
. (162)

while the resolved IEPR is

σρ, j ≡ lim
T →∞

1

T
ln

P
[
(ρt, jt)t∈[0,T ]

]
P
[(
ρT −t,−jT −t

)
t∈[0,T ]

] =〈ˆ drj ·M−1J

〉
. (163)

In this particular case, the decomposition (155) assumed in the general case, can
be proven, as shown in appendix K.2. It leads to the following decomposition of the
Stratonovitch deterministic current:

J(r, [ρ]) =−M(r, [ρ])∇µ(r, [ρ])+JH (r, [ρ]) , (164)

where, for a given ρ, JH is a divergence free vector-field over Rd1. This is the hidden
current, which cannot be estimated from the time-varying density field ρ(r, t) alone,
hence being hidden from the point of view of the sole space F. Using equations (162),
(164), and (160) and integrating by parts gives

σρ =

〈ˆ
drj ·M−1 [−M∇µ]

〉
. (165)

Comparing equations (163) and (165) while taking into account the decomposition of
the current (164), we conclude that the resolved IEPR can indeed be decomposed as
the superposition of the bare and the hidden IEPRs, σρ, j = σρ+σH, where the latter
reads

σH ≡
〈ˆ

drj ·M−1JH

〉
. (166)

Note that, while the hidden current is always divergence free, it depends on the matrix
M: if the latter is varied with a fixed J, then JH changes as well.

5.2.3. Relation to microscopic entropy production. Since we have been considering two
distinct notions of IEPR so far, one could wonder what is the relation between them and
the ‘microscopic’ entropy production, in the case where the field dynamics (150) and
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(151) is explicitly derived from a microscopic one. To answer this question, we consider
an assembly of N interacting particles whose stochastic dynamics reads

ẋi = ã(xi, [ρ̂])+ h̃λ̃+ s̃(ε) (xi, [ρ̂])+ b̃α (xi, [ρ̂]) η̃
α
i , (167)

where xi ∈ Rd1 represents the state of the ith particle, ρ̂(x)≡
∑N

i=1 δ(x−xi) is the empir-
ical measure on the state space Rd1, the η̃i’s are independent Gaussian white noises of

zero mean and variance 〈η̃αi (t)η̃
β
j (t

′)〉= 2δijδ
αβδ(t− t ′), ã and the b̃α’s are vector fields

over Rd1, and h̃λ̃ and s̃(ε) the corresponding λ̃-gauge drift and spurious drift. (A tilde
has been added to every microscopic quantity to avoid any confusion with their field
theoretic counterparts.) Note that a function of N +1 Rd1-variables, f(xi,x1, . . . ,xN ),
can be re-written as f̄(xi, [ρ̂]) iff it is invariant under any permutation of its last N
variables. Physically, this means that the particles in dynamics (167) are identical and
that each of them interact with all the others—itself included—independently of their
label i = 1, . . . ,N . The microscopic IEPR of dynamics (167) reads [15]:

σ̃ =

〈
N∑
i=1

ẋi · D̃
−1
ã(xi, [ρ̂])

〉
, (168)

where D̃≡ b̃b̃
†
is the microscopic diffusion tensor.

Following standard methods [57, 58], dynamics (167) can be shown to give rise to

the stochastic field dynamics (160) and (161), where the mobility reads M= D̃ρ̂ while

the Stratonovitch deterministic current is given by J= ãρ̂− D̃∇ρ̂. Injecting these last
two equalities into the expression of the resolved IEPR (163) gives

σρ̂,̂j =

〈ˆ
ĵ ·
[
D̃

−1
ã−∇ ln ρ̂

]〉
. (169)

Using ∂tρ̂=−∇ · ĵ, the second term on the right-hand side of this last equation reads:

−
〈ˆ

ĵ ·∇ ln ρ̂

〉
=− d

dt

〈ˆ
ρ̂ ln ρ̂

〉
, (170)

and hence vanishes. Finally, as the Stratonovitch empirical current is ĵ≡
∑N

i=1 ẋi δ(x−
xi), we have the equality

σρ̂,̂j = σ̃ . (171)

Thus, for the case considered here, the resolved IEPR (169) of the dynamics of the state-
space empirical measure coincides with the IEPR (168) of the corresponding microscopic
dynamics.
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6. Beyond T-reversal: EMT-reversal

In sections 3–5, we only focused on T-reversal, i.e. on a time reversal that solely amounts
to reversing the time variable. But as explained in the introduction, time reversal of the
dynamics of certain physical systems also requires to flip some degrees of freedom (MT-
reversal), or even directly transform the force-field and the diffusion operator (EMT-
reversal). In [15], we gave explicit conditions for a finite-dimensional dynamics to be
EMT-reversible. In this section, we show how the geometric notations introduced in
section (2) allow us to generalize these conditions to stochastic field dynamics of the
form (8).

To this end, let us first introduce a ‘mirror map’ m[ϕ] that flips some degrees of
freedom. It must be an involution, i.e. such that m[m[ϕ]] = ϕ. We focus here on maps
m that leave the functional Lebesgue measure λ invariant. When that is not the case,
the reversibility conditions given below can be extended and we let the curious reader
adapt for themselves corresponding EMT-reversibility conditions given in [15] for finite-
dimensional dynamics to the current field theoretic setting. We also introduce an ‘exten-
sion map’ e[a,D]≡ (ea[a],eD[D])—which is also an involution—that directly transforms
the drift and diffusion operator.

Denoting by P(a,D) the stationary path-probability of dynamics (8), we can now
define the emt-reversed process of (8): it is the SPDE whose path-probability measure
in steady state, P̄(a,D), is given by

P̄(a,D)

[
(ϕt)t∈T

]
≡ Pe[a,D]

[(
ϕT −t

)
t∈T

]
. (172)

Dynamics (8) is then said to be emt-reversible whenever P̄(a,D) = P(a,D).
We now introduce notations that will be useful below. As in finite dimension, the

mirror map m acts by ‘pushforward’ on the drift a and diffusion operator D respectively
as

(m*a)
ir [ϕ]≡

(
δmir

δϕjr ′ a
jr ′
)
[m(ϕ)] (173)

and

(m*D)i1r1i2r2 [ϕ]≡
(
δmi1r1

δϕi3r3
δmi2r2

δϕi4r4
Di3r3i4r4

)
[m(ϕ)] . (174)

We can then define the symmetric and antisymmetric parts of a and D under the map
m*e:

aS/A ≡ 1

2
(a±m*ea [a]) (175)

and

DS/A ≡ 1

2
(D±m*eD [D]) . (176)
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In the next section, we give three sets of necessary and sufficient conditions for dynam-
ics (8) to be emt-reversible34. These sets of conditions become progressively less general
(for instance the last set of conditions requires D to be invertible while the first does
not), but easier to verify in practice.

6.1. EMT-reversibility conditions

Let us thus start by translating to field-level the most general of the sets of reversibility
conditions found for finite dimensions in [15]. Dynamics (8) is emt-reversible iff there

exist a positive functional P̃ss : F→ R such that

DA = 0 , (177)

aS =Dd ln P̃ss , (178)

div
[
P̃ss

(
a−Dd ln P̃ss

)]
= 0 , (179)

where Dd ln P̃ss is the vector field over F with coordinates Dirjr ′ δ ln P̃ss

δϕjr ′
and div stands for

the functional divergence operator defined in (142). When conditions (177)–(179) are

satisfied, then the functional P̃ss is a35 stationary density (with respect to λ≡Dϕ) of
dynamics (8).

Let us now consider the case where the space F can be decomposed as F= F1×F2

in such a way that the diffusion operator reads

D=

[
0 0
0 D2

]
, (180)

where D2 is invertible on F2. This can apply for instance when the components of ϕ=
(ϕ1,ϕ2) correspond to mass density and velocity, and the mass is conserved. In this case,
the conditions (177)–(179) for dynamics (8) to be emt-reversible can be reformulated as

follows: there exists a positive functional P̃sson F such that

DA
2 = 0 , (181)

aS1 = 0 , (182)

d2D
−1
2 aS2 = 0 , (183)

34 As a reminder, the map t simply transforms a trajectory as m : (ϕt)t∈T 7→ (ϕT −t)t∈T.
35 In section 2, we assumed existence and uniqueness of the stationary probability measure of dynamics (8). All the reversibility
conditions given in this section turn out to be valid even under the weaker assumption that the kernel of the Fokker-Planck operator,
P 7→ −div[aP −DdP ], is one-dimensional. Thus, it also include cases where all the stationary measures are proportional but none
of them is normalized. Note that conditions (177)–(179) are independent of this (positive) proportionality constant between the
various stationary measures.
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a1 · d1 ln P̃ss+ div1 (a1)+ div2
(
aA2
)
+ aA2 ·D−1

2 aS2 = 0 , (184)

where ai is the component of a along the factor Fi, di and divi respectively the exterior
derivative and the divergence operator on Fi. In equation (184), ‘·’ stands for the con-
traction between functional contravariant and covariant tensors over F, i.e. u ·v≡ uirv

ir,
where u and v are covariant and contravariant tensors, respectively36.

Finally, if we consider the case where D is invertible on the whole F, which is
equivalent to the first factor F1 above being reduced to zero, F1 = {0}, then the emt-
reversibility conditions (181)–(184) boil down to

DA = 0 , (185)

dD−1aS = 0 , (186)

div
(
aA
)
+ aA ·D−1aS = 0 . (187)

As in finite dimension, by analogy between the probability and thermodynamical cur-
rents [59], condition (185), which can be reformulated as m*e[D] =D, can be seen as an
Onsager-Casimir symmetry. Then, upon adapting the definition (36) of the ‘t-vorticity’
two-form to define the ‘emt-vorticity’ two-form as

ω ≡ dD−1aS , (188)

condition (186) requires the cancellation of ω, similarly to the T-reversal case. Note
that, although they both belong to Ω2(F), these t- and emt-vorticities are distinct in gen-
eral. Finally, in the case of condition (187), a satisfying physical interpretation remains
elusive, as is also the case for its finite-dimensional counterpart [15].

As compared to the two others, the third set of reversibility conditions (185)–(187)
requires the strongest assumption: the invertibility of D on the whole F. But, as in finite
dimension, it remarkably does not refer to any unknown functional P̃ss, as opposed
to conditions (177)–(179) or (181)–(184). On the other hand, contrary to the finite-
dimensional setting, it does not imply that conditions (185)–(187) can always be easily
checked in practice, as they require either the explicit knowledge of the inverse of the
operator D, or the symmetric drift to be decomposed as aS =DαS with αS explicitly
known. When it is not the case, D−1aS is not explicitly known and, in particular, a
major part of the agenda established in part I is consequently blocked. Finally, an addi-
tional difficulty of these three sets of reversibility conditions, inherent to our functional
setting, is that they involve the functional divergence operator div that often produces
singularities.

36 We did not write the ‘·’ explicitly between D−1
2 and aS2 to lighten notations, having also in mind that this abuse of notation

draws an analogy with matrix multiplication.
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6.2. New sources of entropy production and topology

In this section, we focus on the case where D is invertible on F. For given maps e &
m, the (bare) emt-IEPR, i.e. the IEPR that quantifies the breakdown or otherwise of
emt-reversal of dynamics (8), is defined as

σ ≡ lim
T →∞

1

T
ln

P(a,D)

[
(ϕt)t∈T

]
P̄(a,D)

[
(ϕt)t∈T

] . (189)

When the Onsager-Casimir condition (185) is satisfied, directly generalizing a result
of [15] (and equation (143)), we conclude that this (emt-) IEPR reads:

σ =
1

2

ˆ
F
C ·ω Dϕ−

ˆ
F

[
div
(
aA
)
+ aA ·D−1aS

]
PssDϕ , (190)

where ω is the emt-vorticity two-form (188), PssDϕ the stationary measure, and
C ·ω ≡ Cirjr ′

ωirjr ′ = Cirjr ′
[dD−1aS]irjr ′, with C a functional, contravariant, antisym-

metric tensor of order two whose divergence equals the negative of the stationary
probability current, div(C) =−Jss. Because EMT-reversibility is both equivalent to
conditions (185)–(187) and to σ=0, we conclude that dynamics (8) is reversible iff
the two integrals in (190) vanish independently. Consequently, the left-hand side of
equation (187) and that of equation (186) (the emt-vorticity two-form) can be seen as
two independent and additive sources of entropy production. Further, these sources are
different in their mathematical nature are they are respectively a scalar field and a
two-form over F. Note that this differs from the simplest case of T-reversal, where there
can be an entropy source of only one type: the (T-) vorticity two-form (36) – the latter
being generically distinct from the emt-vorticity two-form (188) for non trivial mirror
(m) and extension (e) maps. It is also worth noting that going from a pair of maps (m,e)
to another one changes the decomposition a= aS + aA by transferring terms between
symmetric and antisymmetric components, and hence modifies the IEPR by altering
the two integrals in equation (190).

Finally note that condition (186) is equivalent to the functional one-form being closed
and therefore exact since we have been assuming the space F to be simply connected
throughout this article. When this topological assumption does not hold, condition (186)
(and similarly condition (183)) must be augmented with topological constraints, as in
finite dimension [15]. More precisely, when F is not simply connected, condition (186)
should be replaced by:

dD−1aS = 0 and, ∀i = 1, . . . ,dim(H1 (F)) ,
ˆ
Ci
D−1aS = 0 , (191)

where {Ci}i is a set of loops in F, generating its first homology group H1(F), along
which we integrate the functional one-form D−1aS. Intuitively, the first part of condi-
tion (191) forbids the one-form D−1aS to rotate around any point in F, while its second
part prevents rotations around any holes of F. When H1(F) is not trivial, i.e. when F
is not simply-connected, additional entropy production terms, that accounts for this
topological obstruction to EMT-reversibility, must be added to the right-hand side of
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equation (190). Assuming that Hodge-de Rham theory [55] can be extended to infinite
dimensional manifolds (which as far as we know remains unproven), the stationary prob-

ability current, which is divergence-free, can be written Jss =−divC+
∑dim(H1(F))

α=1 jαγα,
where (γα)α=1,...,dim(H1(F)) is a basis of harmonic vector fields on F. It follows (see [15]
for details in the finite-dimensional counterpart) that the IEPR reads:

σ =
1

2

ˆ
F
C ·ω Dϕ+

dim(H1(F))∑
α=1

jα
ˆ
γα ·D−1aSDϕ

−
ˆ
F

[
div
(
aA
)
+ aA ·D−1aS

]
PssDϕ , (192)

with γα ·D−1aS ≡ γirα [D
−1aS]ir. Once again, and for the same reason as above, these

topological terms in the expression (192) of σ can be interpreted as additional inde-
pendent sources of entropy production.

If the target space N of ϕ is a vector space, then F is also a vector space. In
this case, F is simply connected, and there cannot be any topological obstruction to
the reversibility of (8). However, as soon as H1(N ) is non-trivial—which is often the
case when the field ϕ is a Goldstone mode associated with a continuous symmetry
spontaneously broken, for instance—one can expect H1(F) to also be non-trivial. In
such a case, if the system is out of equilibrium, there may exist a ‘force’ that tends to
continuously drive the field along loops in H1(N ), thereby creating a topological source
of irreversibility.

Examples of systems where such a topological obstruction to reversibility can arise
are abundant in statistical physics, ranging from continuous versions of the Kuramoto
model [60–63], a paradigmatic model of synchronization between coupled oscillators, to
chiral active systems [64–68], as well as pulsatile active matter [69–71].

7. Conclusion

In this article we introduced a functional geometric formalism that allowed us to gen-
eralize to stochastic field dynamics various results that were previously only known
for finite dimensional systems (notably in sections 3, 5.1 and 6). In particular, for
stochastic field theories governed by (8) we gave fully general reversibility conditions
for both standard time reversal symmetry (T-reversibility) and its extended counterpart
(EMT-reversibility). In each case we showed how these yield simpler conditions under
the assumption of partial or complete invertibility of the diffusion operator D. These
results generalize those we presented in part I [15] for finite dimensional dynamics, and,
to the best of our knowledge, were unknown previously for fields even in the simplest
case of T-reversibility.

Most of the work presented in this article focused on the latter, simplest notion of
time reversal. Building on the insights first presented in [14], we showed T-reversibility
to be equivalent to the cancellation of the vorticity two-form ω. Contrary to its finite
dimensional counterpart, this T-reversibility criterion is distributional (i.e. it amounts
to the cancellation of a distribution) and can thus be hard to make use of. We fully
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solved this problem in the local, one-spatial-dimension case by constructing a basis of
two-forms that turns the distributional condition into an easily applicable algebraic one.

Further, when the dynamics is irreversible, we showed how one can gain insight into
the corresponding nonequilibrium phenomenology through the flow (47) of the vorticity
operator, the latter being dual to the vorticity two-form. By examining in this way
the phenomenology associated to the elements of the aforementioned basis, we found
that they can be divided into three subfamilies, with the elements of each subfamily
exhibiting closely related, characteristic phenomenologies. We demonstrated that many
well-known, typically out-of-equilibrium phenomena, such as flocking and those induced
by non-reciprocal interactions, can be classified in this manner, their respective vorticity
two-forms each belonging to a specified subspace of the decomposition (87) of the space
of two-forms Ω2(F).

At the end of section 4, we discussed in detail how this decomposition of Ω2(F)
extends to more general contexts and take the form (135), the additional factors of the
decomposition presumably accounting for e.g. the notoriously rich boundary effects of
active systems. We also discussed how this decomposition might be used to build field
theories with desired properties.

In section 5, we studied the relation between entropy production and vorticity. In
particular we showed the loop-wise entropy production and informatic entropy produc-
tion rate (IEPR) to both be linear functionals of ω. While the relation with the loop-wise
entropy production gives another connection between ω and the generic nonequilibrium
phenomenology of the dynamics, as demonstrated in section 5.1.3, the link we establish
to the IEPR allows the elements of the decomposition (135) of Ω2(F) to be interpreted
as independent sources of entropy production. We also showed that hidden currents
and a resulting contribution to IEPR can arise, typically when the field ϕ is conserved.
They are hidden from the space F in the sense that there presence is only revealed by
considering the joint statistics of the field and its corresponding current.

Finally, in section 6, we gave reversibility conditions for arbitrary EMT-reversal
rather than the simple T-reversal considered up to that point. We showed that con-
sidering nontrivial mirror (m) and extension (e) maps—which respectively flip the odd
parts of the degrees of freedom, drift, and diffusion operator under time-reversal—leads
to a corresponding emt-IEPR that is the superposition of several independent sources
of entropy production, including the (emt-)vorticity two-form, while the (T-)voticity
two-form is the unique source for T-irreversibility. Similarly, additional sources arise if
the space F to which ϕ belongs is not simply connected. Studying all these additional
irreversibility sources in a way that is similar to what we did for the vorticity space
in this article is an exciting challenge for the future that could move towards a more
complete classification of out-of-equilibrium field theories by precisely characterizing
their irreversibility and showing how it links to qualitatively as well as quantitatively
observable features.
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Appendix A. An ill–defined spurious drift

In this appendix, we compute the spurious drift

sr1(ε) ≡
δ

δϕr3
br1ir2b

r3
ir2

− 2εbr3ir2
δ

δϕr3
br1ir2 , (193)

associated to the operator

brjr ′ =
√
M (ϕ(r ′))∂r′jδ (r− r ′) . (194)

The first term of the above expression of sr1(ε) reads

δ

δϕr3
br1ir2b

r3
ir2

=
∑
i

ˆ
dr2dr3

[
∂ri2δ (r1− r2)

][
∂ri2δ (r3− r2)

] δ

δϕr3
M (ϕr2)

=
∑
i

ˆ
dr2dr3

[
∂ri2δ (r1− r2)

][
−∂ri3δ (r3− r2)

] δ

δϕr3
M (ϕr2)

=
∑
i

ˆ
dr2

[
∂ri2δ (r1− r2)

] [
∂ri3
δM (ϕr2)

δϕr3

]∣∣∣∣
r3=r2

,

where we have used that ∂ri2δ(r3− r2) =−∂ri3δ(r3− r2) to go from the first to the second
line, and did an integration by parts to get to the last line.

Similarly, the second term in the expression of s(ε) reads

−2εbr3ir2
δ

δϕr3
br1ir2 =−2ε

∑
i

ˆ
dr2dr3

[
∂ri2δ (r1− r2)

][
∂ri2δ (r3− r2)

]√
M (ϕr2)

δ

δϕr3

√
M (ϕr2)

=−ε
∑
i

ˆ
dr2dr3

[
∂ri2δ (r1− r2)

][
∂ri2δ (r3− r2)

] δ

δϕr3
M (ϕr2) ,

which is −ε times the first term. The total spurious drift is thus

sr1(ε) = (1− ε)
∑
i

ˆ
dr2

[
∂ri2δ (r1− r2)

] [
∂ri3
δM (ϕr2)

δϕr3

]∣∣∣∣
r3=r2

. (195)

This is ill-defined as described in the main text (equation (14)).

Appendix B. Functional stokes theorem

Let S ⊂ F be a smooth, connected, and oriented surface in the function space F, whose
(smooth oriented) boundary is denoted by ∂S. Let ζ be a functional one–form over
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F. The objective of this appendix is to show that Stokes’ theorem37 still holds in the
functional space F, namely that we have

ˆ
∂S

ζ =

ˆ
S

dζ . (196)

To prove this, we can show that the functional exterior derivative d is well behaved with
respect to the pullback. We will then only need to use the finite–dimensional Stokes’
theorem.

We start by assuming that we can parametrize the suface S by another smooth, con-
nected, and oriented surface s⊂ R2, through a diffeomorphism Φ : R2 → F, i.e. Φ(s) = S.

On the one hand, the change of variable formula38 first gives
ˆ
∂S

ζ =

ˆ
∂s

Φ*ζ , (197)

where Φ* stands for the pullback with respect to the map Φ (whose definition is recalled
below). But Φ*ζ is then nothing but a usual one–form on R2, to which we can apply
the (finite dimensional) Stokes’ theorem, namely

ˆ
∂s

Φ*ζ =

ˆ
s

d
(
Φ*ζ

)
, (198)

where d stands for the finite dimensional exterior derivative.
On the other hand, the change of variables formula similarly gives for two–forms:

ˆ
S

dζ =
ˆ
s

Φ* (dζ) . (199)

Hence, if we can show that the pullback commutes with the exterior derivatives (the
usual one, and the functional one), i.e. that

ˆ
s

d
(
Φ*ζ

)
=

ˆ
s

Φ* (dζ) , (200)

then we will be able to conclude from equations (197)–(200) that the functional Stokes’
theorem (196) does hold.

We thus turn to the proof of equation (200). In order to avoid any confusion with
the spatial variable r of the fields ϕ(r) that belong to F, let us denote by (t,τ) the
canonical coordinates of R2, rather than by (x, y).

We first evaluate the pullback by Φ of the functional exterior derivative dζϕ =
δζjr ′

δϕir [ϕ]δ
ir ∧ δjr ′

, of ζϕ = ζir[ϕ]δ
ir on a pair of vectors u= ut∂t+uτ∂τ and v= vt∂t+ vτ∂τ

37 We here only give a proof for one-forms and their functional exterior derivatives, but it can be easily adapted to show that the
functional Stokes’ theorem actually holds for functional differential forms of any order.
38 Note that formula (197) could actually be used as the definition of the integral of a functional one–form ζ on a smooth line in F.
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at an arbitrary point (t,τ) ∈ s:[
Φ*dζ

]
(t,τ)

(u,v) =
δζjr ′

δϕir
[Φ(t,τ)]δir ∧ δjr ′

(dΦ(u) ,dΦ(v)) . (201)

Using the expression of the differential dΦ = ∂tΦdt+ ∂τΦdτ of Φ together with the
bilinearity of the skew–symmetry map δir ∧ δjr ′

, we get

[
Φ*dζ

]
(t,τ)

(u,v) =
δζjr ′

δϕir
[Φ(t,τ)]

{[
∂tΦ

irut+ ∂τΦ
iruτ

][
∂tΦ

jr ′
vt+ ∂τΦ

jr ′
vτ
]

(202)

−
[
∂tΦ

jr ′
ut+ ∂τΦ

jr ′
uτ
][
∂tΦ

irvt+ ∂τΦ
irvτ
]}

(203)

=
δζjr ′

δϕir
[Φ(t,τ)]

[(
∂tΦ

ir
)(
∂τΦ

jr ′
)
−
(
∂tΦ

jr ′
)(
∂τΦ

ir
)][

utvτ −uτvt
]
.

(204)

In terms of two–forms, this also reads

[
Φ*dζ

]
(t,τ)

=
δζjr ′

δϕir
[Φ(t,τ)]

[(
∂tΦ

ir
)(
∂τΦ

jr ′
)
−
(
∂tΦ

jr ′
)(
∂τΦ

ir
)]

dt∧dτ . (205)

Let us now turn to the evaluation on (u,v) of the (finite–dimensional) exterior
derivative of Φ*ζ. We first have that the pullback Φ*ζ applied to u reads[

Φ*ζ
]
(t,τ)

(u) = ζir [Φ(t,τ)]δir [dΦ(u)] = ζir [Φ(t,τ)]
[
ut∂tΦ

ir+uτ∂τΦ
ir
]
, (206)

where we just used the linearity of δir. In terms of one–forms, it reads[
Φ*ζ

]
(t,τ)

= ζir [Φ(t,τ)]
[
∂tΦ

irdt+ ∂τΦ
irdτ

]
. (207)

We can then easily compute the exterior derivative[
d
(
Φ*ζ

)]
(t,τ)

= ∂τ
{
ζir [Φ(t,τ)]∂tΦ

ir
}
dτ ∧dt+ ∂t

{
ζir [Φ(t,τ)]∂τΦ

ir
}
dt∧dτ . (208)

Using the chain rule together with the skew–symmetry property dτ ∧dt=−dt∧dτ , we
get [

d
(
Φ*ζ

)]
(t,τ)

=
δζir
δϕjr ′

[
∂tΦ

jr ′
∂τΦ

ir− ∂τΦ
jr ′
∂tΦ

ir
]
dt∧dτ , (209)

which coincides with the right–hand side of equation (205). Thus, we showed that
Φ*dζ = d(Φ*ζ), consequently that equation (200) holds, and finally that the functional
Stokes’ theorem (196) follows.
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Appendix C. Vorticity of the active model B

The vorticity of AMB (19) and (20) was previously computed by one of us in [14] using
a less general version of definition (26). In this appendix, for illustrative purposes, we
rederive expression (37) for ω using a slightly different approach—namely, formula (32)
– which allows us to compute the exterior derivative directly at the level of functional
forms, without introducing any pair of perturbations (δρ1,δρ2). For completeness, we
also derive expression (62) for the corresponding vorticity operator.

The following calculation involves two integration variables, denoted r and r ′, and
the integrals are written out explicitly for clarity—that is, without using the general-
ized Einstein summation convention introduced in section 2.2. Although not written
explicitly to keep the notation light, the field ρ and its derivatives are always evaluated
at point r, not at r ′, and the functions λ and κ are evaluated at ρ(r).

As shown at the end of section 2.2 and further discussed in section 3.1, in the case
of AMB:

D−1a=−
ˆ

drµrδ
r . (210)

Hence, using equation (32), we get

ω ≡ dD−1a=−d

[ˆ
drµrδ

r

]
=−
ˆ

dr d [µr]∧ δr =−
ˆ

drdr ′ δµr

δρr ′ δ
r ′ ∧ δr (211)

Now, the functional derivative of µ reads

δµr

δρr ′ =
[
a+2bρ+λ ′|∇ρ|2−κ ′∆ρ

]
δ (r− r ′)+ 2λ∇ρ ·∇rδ (r− r ′)−κ∆rδ (r− r ′)

=
[
a+2bρ+λ ′|∇ρ|2−κ ′∆ρ

]
δ (r− r ′)− 2λ∇ρ ·∇r ′δ (r− r ′)−κ∆r ′δ (r− r ′) ,

where we used ∇rδ(r− r ′) =−∇r ′δ(r− r ′) to go from the first line to the second.
Injecting this in the expression (211) of the vorticity yields

ω =−
ˆ

dr
[
a+2bρ+λ ′|∇ρ|2−κ ′∆ρ

]
δr ∧ δr

+

ˆ
drdr ′ [2λ∇ρ ·∇r ′δ (r− r ′)+κ∆r ′δ (r− r ′)]δr

′ ∧ δr . (212)

Since the wedge product is antisymmetric, δr ∧ δr = 0, and the first line on the right-
hand side of equation (212) vanishes. Integrating by parts then gives

ω = −
ˆ

drdr ′δ (r− r ′)
[
2λ∇ρ ·∇r ′

(
δr

′ ∧ δr
)
−κ∆r ′

(
δr

′ ∧ δr
)]

= −
ˆ

drdr ′δ (r− r ′)
[
2λ∇ρ ·

(
−∇δr ′

)
∧ δr−κ

(
∆δr

′
)
∧ δr

]
,

where the second line is due to the convention ∇r ′
[
δr

′ ∧ δr
]
(δρ1,δρ2)≡

∇r ′
[
δρr

′
1 δρ

r
2− δρr1δρ

r ′
2

]
= δρr2∇δρr

′
1 − δρr1∇δρr

′
2 , while

[
∇δr ′]∧ δr(δρ1,δρ2)≡
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[
∇δr ′

(δρ1)
]
δr(δρ2)−

[
∇δr ′

(δρ2)
]
δr(δρ1) =

[
−∇δρr ′

1

]
δρr2−

[
−∇δρr ′

2

]
δρr1 = δρr1∇δρr

′
2 −

δρr2∇δρr
′

1 , the sign difference arising from the definition of the Dirac-delta gradient.
Integrating out r ′, and using the skew-symmetry of the wedge product, the vorticity
reads

ω = −
ˆ

dr [2λ∇ρ · (−∇δr)∧ δr−κ(∆δr)∧ δr]

= −
ˆ

dr [2λ∇ρ · δr ∧∇δr+κδr ∧∆δr] .

Finally, using equation (68), and integrating by parts yields the formula we wanted to
prove:

ω =−
ˆ

dr [2λ+κ ′]∇ρ · δr ∧∇δr . (213)

Let us now turn to the vorticity operator W and show that it is given by
equation (62) in the case of AMB. We start by deriving the expression for the cor-
responding cycle affinity operator ω̂. To do so, we first apply the vorticity 2-form (213)
to a pair of fluctuations (δρ1,δρ2) and integrate by parts to factorize δρ1 on the left-hand
side of the integral:

ωρ (δρ1,δρ2) =

ˆ
dr (2λ+κ ′)∇ρ · [δρ1∇δρ2− δρ2∇δρ1]

=

ˆ
drδρ1 {(2λ+κ ′)∇ρ ·∇δρ2+∇· [δρ2 (2λ+κ ′)∇ρ]} .

Using definition (39), we then identify the curly bracket in this last integral as ω̂ρδρ2.
Applying formula (46), with D=−M∆ for AMB, finally yield the desired expression
for the vorticity operator:

Wρδρ=
M

2
∆{(2λ+κ ′)∇ρ ·∇δρ+∇· [δρ(2λ+κ ′)∇ρ]} . (214)

Appendix D. Intermediate results about polynomials and antisymmetric
differential operators

The objective of this appendix is to show that the operators

DA
k : H×H −→ H and DS

k : H×H −→ H
(ψ1,ψ2) 7−→ ψ2∂

kψ1−ψ1∂
kψ2 (ψ1,ψ2) 7−→ ψ2∂

kψ1 +ψ1∂
kψ2
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which are, up to a factor 2, respectively the skewsymmetric and symmetric part of the
operators

Dk : H×H −→ H
(ψ1,ψ2) 7−→ ψ2(x)∂

kψ1(x)

where H is the space of smooth functions from R to itself, can be decomposed in the
following way:

∀j DA
2j =

j−1∑
i=0

b2j2i+1∂
(2j−2i−1)DA

2i+1 , (215)

∀j DS
2j+1 =

j∑
i=0

c2j+1
2i ∂(2j+1−2i)DS

2i , (216)

where the coefficients b2j2i+1 and c2j+1
2i and recursively defined through:

∀j ∈ N*,∀i < j, b2j2i+1 = a2j2i+1+

j−1∑
k=i+1

a2j2kb
2k
2i+1 , (217)

and ∀j ∈ N,∀i⩽ j, c2j+1
2i = a2j+1

2i +

j−1∑
k=i

,a2j+1
2k+1c

2k+1
2i (218)

with ank =
(−1)n−1−k

2

(
n

k

)
. (219)

To this end, we first show in section D.1 a similar factorization for some polynomials in
R[X,Y ]. Then, thanks to an algebra isomorphism between R[X,Y ] and an appropriate
algebra of operators, we deduce in section D.2 the above formula.

D.1. Factorization of polynomials

The objective of this section is to prove lemma 2 below. We will first prove the prelim-
inary lemma 1.

Lemma 1. For any integer n,
– if n is even:

Xn−Y n =
n−1∑
k=0

ank (X +Y )n−k
(
Xk−Y k

)
, (220)

– if n is odd:

Xn+Y n =
n−1∑
k=0

ank (X +Y )n−k
(
Xk+Y k

)
, (221)
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with

ank ≡
(−1)n+k+1

2

(
n

k

)
. (222)

Proof. Let us consider an arbitrary natural number n, and two unknown variables X
and Y. Using the binomial formula, we get :

Xn+Y n = [(X +Y )−Y ]n+ [(X +Y )−X]n

=
n∑
k=0

(
n

k

)
(X +Y )n−k (−1)k

(
Xk+Y k

)
.

Moving the k =n term to the right hand side of the equality leads to

(Xn+Y n)(1− (−1)n) =
n−1∑
k=0

(
n

k

)
(X +Y )n−k (−1)k

(
Xk+Y k

)
. (223)

Hence, for n odd, we get

Xn+Y n =
n−1∑
k=0

(−1)k

2

(
n

k

)
(X +Y )n−k

(
Xk+Y k

)
. (224)

Similarly, we have

Xn−Y n = [(X +Y )−Y ]n− [(X +Y )−X]n

=
n∑
k=0

(
n

k

)
(X +Y )n−k (−1)k+1 (Xk−Y k

)
,

i.e.

(Xn−Y n)
(
1− (−1)n+1

)
=

n−1∑
k=0

(−1)k+1

(
n

k

)
(X +Y )n−k

(
Xk−Y k

)
. (225)

Thus, when n is even

(Xn−Y n) =
n−1∑
k=0

(−1)k+1

2

(
n

k

)
(X +Y )n−k

(
Xk−Y k

)
. (226)

Introducing the coefficient ank , defined by equation (222), allows to recover the two
formulas we had to prove.

Lemma 2. For any j ∈ N, we have the factorizations:

X2j −Y 2j =

j−1∑
i=0

b2j2i+1 (X +Y )2j−2i−1 (X2i+1−Y 2i+1
)
, (227)

and X2j+1+Y 2j+1 =

j∑
i=0

c2j+1
2i (X +Y )2j+1−2i (X2i+Y 2i

)
, (228)
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where the coefficients b2j2i+1 and c2j+1
2i are recursively defined through:

∀j ∈ N*,∀i < j, b2j2i+1 ≡ a2j2i+1+

j−1∑
k=i+1

a2j2kb
2k
2i+1 , (229)

and ∀j ∈ N,∀i⩽ j, c2j+1
2i ≡ a2j+1

2i +

j−1∑
k=i

a2j+1
2k+1c

2k+1
2i , (230)

with ank =
(−1)n+k+1

2

(
n

k

)
. (231)

Proof. Again, we only prove the odd case, the even case being proved in the same way.
We make the proof through strong induction. The first step j =0 gives 0 = 0, which is
true. We then choose j ∈ N. We assume the lemma to be true ∀i < j. We prove it for j,
using lemma 1 and then the recurrence hypothesis:

X2j −Y 2j =

2j−1∑
i=0

a2ji (X +Y )2j−i
(
X i−Y i

)
=

j−1∑
k=0

a2j2k (X +Y )2j−2k (X2k−Y 2k
)
+

j−1∑
k=0

a2j2k+1 (X +Y )2j−(2k+1) (X2k+1−Y 2k+1
)

=

j−1∑
k=0

a2j2k (X +Y )2j−2k
k−1∑
i=0

b2k2i+1 (X +Y )2k−2i−1 (X2i+1−Y 2i+1
)

+

j−1∑
i=0

a2j2i+1 (X +Y )2j−(2i+1) (X2i+1−Y 2i+1
)

=

j−1∑
i=0

(
j−1∑
k=i+1

a2j2kb
2k
2i+1

)
(X +Y )2j−2i−1 (X2i+1−Y 2i+1

)
+

j−1∑
i=0

a2j2i+1 (X +Y )2j−2i−1 (X2i+1−Y 2i+1
)

=

j−1∑
i=0

(
a2j2i+1 +

j−1∑
k=i+1

a2j2kb
2k
2i+1

)
(X +Y )2j−2i−1 (X2i+1−Y 2i+1

)
.

D.2. Algebra of operators and algebra isomorphism

An important problem that we face from the beginning is that if we treat the operators

Dk : H×H −→ H
(ψ1,ψ2) 7−→ ψ2(x)∂

kψ1(x)
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directly, we will not be able to compose them, which is not ideal to solve a factorization
problem. Hence, we are going to consider first the lifted operators:

D̃k : H×H −→ H⊗H
(ψ1,ψ2) 7−→ ∂kψ1⊗ψ2

where ψ2⊗ ∂kψ1 : (x,y) 7→ ψ2(x)∂
kψ1(y) is the tensor product of functions ψ2 and ∂

kψ1.

We recover Dk from D̃k using the linear projection:

πH : H⊗H −→ H
f(x,y) 7−→ πH(f )(x)≡ f(x,x) .

Indeed

Dk = πH ◦ D̃k , (232)

where ◦ denotes the composition. We note that, since the operators D̃k are bilinear,
they factorize through ⊗ in a unique way. In other words, the fundamental property of
the tensor product ensures the existence, for all integer k, of a unique operator D̄k

D̄k : H⊗H −→ H⊗H
f(x,y) 7−→ ∂kxf(x,y).

We can now work with the operators D̄k that are endomorphisms of H⊗H, i.e.
D̄k ∈ End(H⊗H). Moreover, they can be written as

D̄k = ∂k⊗ idH , (233)

where idH is the identity of End(H). The transitions between the different spaces is
summarized in the following commutative diagram.

The other crucial point of this change of space is that the derivation operator ∂ ≡ d
dx

of H corresponds in H⊗H to the operator ∂⊗ idH+ idH⊗ ∂ in the sense that

d

dx
= πH ◦ (∂⊗ idH+ idH⊗ ∂) . (234)
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Indeed

[πH ◦ (∂⊗ idH+ idH⊗ ∂)] (ψ1⊗ψ2)(x) =

ˆ
[∂xψ1 (x)ψ2 (y)+ψ1 (x)∂yψ2 (y)]δ (x− y)dy

= ψ2 (x)∂xψ1 (x)+ψ1 (x)∂xψ2 (x)

=
d

dx
(ψ1 (x)ψ2 (x)) .

More generally, it can be shown that

dk

dxk
= πH ◦ (∂⊗ idH+ idH⊗ ∂)k . (235)

We can now prove the factorization announced at the beginning of this appendix by
using the factorization of polynomials shown in section D.1. To do so, we first defined
the operators:

D̄A
k : H⊗H −→ H⊗H

ψ1⊗ψ2 7−→ ∂kψ1⊗ψ2−ψ1⊗ ∂kψ2

and

D̄S
k : H⊗H −→ H⊗H

ψ1⊗ψ2 7−→ ∂kψ1⊗ψ2+ψ1⊗ ∂kψ2

or in other words

D̄A
k = ∂k⊗ idH− idH⊗ ∂k and D̄S

k = ∂k⊗ idH+ idH⊗ ∂k . (236)

Let us denote by A the subalgebra of End(H⊗H) generated by the families (DA
k ,DS

k )k∈N.
The algebra (A,+, ·,◦), where +, · and ◦ are respectively the sum of operators, the
product by a real number, and the composition of operators, is a commutative algebra
made out of elements of the form∑

k,n

λk,n∂
k⊗ ∂n , (237)

where the sum is over a finite set of natural integers and λk,n ∈ R. We then define the
map

Λ : A→ R [X,Y ] (238)

such that for any pair of natural numbers (k,n)

Λ
((
∂k⊗ idH

)
◦ (idH⊗ ∂n)

)
= Λ

(
∂k⊗ ∂n

)
≡XkY n (239)

that we extend by linearity to the full algebra A. Note that the first equality in the
definition of Λ has been explicitly written down to insist on the fact that it is the
composition in A that corresponds to the product in R[X,Y ] and not the tensor product.
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The important point here is that Λ is an algebra isomorphism since it is a morphism
that sends a basis of A (the family (∂k⊗ ∂n)k,n∈N) to the canonical basis of R[X,Y ].
Thus applying the map πH ◦Λ−1 to the factorization formula of lemma 2 allows us to
complete the proof.

Indeed, by first applying Λ−1 to equations (227) and (228) of lemma 2, we get that
for all natural numbers j :

∂2j ⊗ idH− idH⊗ ∂2j =

j−1∑
i=0

b2j2i+1 [(∂⊗ idH)+ (idH⊗ ∂)]2j−2i−1

◦
[
∂2i+1⊗ idH− idH⊗ ∂2i+1

]
(240)

and

∂2j+1⊗ idH+ idH⊗ ∂2j+1 =

j∑
i=0

c2j+1
2i [(∂⊗ idH)+ (idH⊗ ∂)]2j+1−2i

◦
[
∂2i⊗ idH+ idH⊗ ∂2i

]
. (241)

Besides, for any k and n:[
πH ◦ [(∂⊗ idH)+ (idH⊗ ∂)]k ◦ [∂n⊗ idH± idH⊗ ∂n]

]
(ψ1,ψ2)(x)

=
[
πH ◦ [(∂⊗ idH)+ (idH⊗ ∂)]k

]
(∂nψ1⊗ψ2±ψ1⊗ ∂nψ2)(x)

=
dk

dxk
(ψ2 (x)∂

nψ1 (x)±ψ1 (x)∂
nψ2 (x))

=
dk

dxk
DS,A
n (ψ1,ψ2)(x) .

Thus, applying πH to formulas (240) and (241) finally yields:

DA
2j =

j−1∑
i=0

b2j2i+1

d(2j−2i−1)

dx(2j−2i−1)
DA

2i+1 (242)

and

DS
2j+1 =

j∑
i=0

c2j+1
2i

d(2j+1−2i)

dx(2j+1−2i)
DS

2i (243)

where the coefficients bnk and cnk are those of lemma 2.

Appendix E. A basis of 2-forms in d 1 = 1 spatial dimension

The objective of this appendix is to show that the family (78) is a basis of the space
Ω2

loc(F) in d1=1 spatial dimension. To lighten notations, we will rather denote a fluc-
tuation δϕ by ψ.
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E.1. A generative family of local two-forms

In this subsection, we show that the family (78) generates the space Ω2
loc(F). To this

end, let us consider a local two-form γ ∈ Ω2
loc(F). It generically reads

γ =

q∑
k=0

γ
(k)
ijxδ

ix ∧ ∂kδjx , (244)

for some natural number q, where we implicitly sum over i,j ∈ {1, . . . ,d2} and integ-
rate over x ∈ R. We introduce the symmetric and antisymmetric parts of the matrices

γ(k)(x, [ϕ]), which are given by S/Aγ
(k)
ij ≡ (γ

(k)
ij ± γ

(k)
ji )/2. Distinguishing symmetric from

antisymmetric parts of each γ(k) and separating odd and even degree derivatives in (244)
gives:

γ =

bq/2c∑
ℓ=0

[
Sγ

(2ℓ)
ijx + Aγ

(2ℓ)
ijx

]
δix ∧ ∂2ℓδjx+

b(q−1)/2c∑
ℓ=0

[
Sγ

(2ℓ+1)
ijx + Aγ

(2ℓ+1)
ijx

]
δix ∧ ∂2ℓ+1δjx. (245)

For each implicit sum over i,j = {1, . . . ,d2} above, we add a copy of it where the dummy
indices are exchanged i↔ j, and divide everything by two so that the overall quantity
is unchanged. Using the (anti)symmetry of A/Sγ(k), we get

γ =
1

2

bq/2c∑
ℓ=0

{
Sγ

(2ℓ)
ijx

[
δix ∧ ∂2ℓδjx+ δjx ∧ ∂2ℓδix

]
+ Aγ

(2ℓ)
ijx

[
δix ∧ ∂2ℓδjx− δjx ∧ ∂2ℓδix

]}

+
1

2

b(q−1)/2c∑
ℓ=0

{
Sγ

(2ℓ+1)
ijx

[
δix ∧ ∂2ℓ+1δjx+ δjx ∧ ∂2ℓ+1δix

]
+ Aγ

(2ℓ+1)
ijx

[
δix ∧ ∂2ℓ+1δjx− δjx ∧ ∂2ℓ+1δix

]}
. (246)

We see that the terms proportional to Aγ
(2ℓ)
ijx and Sγ

(2ℓ+1)
ijx are already decomposed in the

basis (78). In what follows, we show that the other terms can be decomposed as well
in that basis. Let us start by relating the elementary two-forms in (246) that do not

belong to the basis (78) to the differential operator DS/A
k defined in appendix D. For

any pair ϕ1,ψ2 of perturbations and any natural number k, we have[
δi ∧ ∂kδj ± δj ∧ ∂kδi

]
(ψ1,ψ2) = (−1)k

{[
ψi1∂

kψj2 −ψi2∂
kψj1

]
±
[
ψj1∂

kψi2−ψj2∂
kψi1

]}
= (−1)k

{[
ψi1∂

kψj2 ∓ψj2∂
kψi1

]
±
[
ψj1∂

kψi2 ∓ψi2∂
kψj1

]}
,

where we simply rearranged the terms. Consequently, using the definitions of DS/A
k from

appendix D, we have the relation
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[
δi ∧ ∂kδj ± δj ∧ ∂kδi

]
(ψ1,ψ2) = (−1)k

{
DA/S
k

(
ψj2,ψ

i
1

)
±DA/S

k

(
ψi2,ψ

j
1

)}
. (247)

Using this relation together with decomposition (242) on the one hand, we have:[
δi ∧ ∂2ℓδj + δj ∧ ∂2ℓδi

]
(ψ1,ψ2) =DA

2ℓ

(
ψj2,ψ

i
1

)
+DA

2ℓ

(
ψi2,ψ

j
1

)
=

ℓ−1∑
k=0

b2ℓ2k+1∂
2ℓ−2k−1
x

[
DA

2k+1

(
ψj2,ψ

i
1

)
+DA

2k+1

(
ψi2,ψ

j
1

)]
= −

ℓ−1∑
k=0

b2ℓ2k+1∂
2ℓ−2k−1
x

{[
δi ∧ ∂2k+1δj + δj ∧ ∂2k+1δi

]
(ψ1,ψ2)

}
,

i.e.

δi ∧ ∂2ℓδj + δj ∧ ∂2ℓδi =−
ℓ−1∑
k=0

b2ℓ2k+1∂
2ℓ−2k−1
x

[
δi ∧ ∂2k+1δj + δj ∧ ∂2k+1δi

]
. (248)

On the other hand, using (247) and (243) gives:[
δi ∧ ∂2ℓ+1δj − δj ∧ ∂2ℓ+1δi

]
(ψ1,ψ2) = −DS

2ℓ+1

(
ψj2,ψ

i
1

)
+DS

2ℓ+1

(
ψi2,ψ

j
1

)
=

ℓ∑
k=0

c2ℓ+1
2k ∂2ℓ−2k+1

x

[
−DS

2k

(
ψj2,ψ

i
1

)
+DS

2k

(
ψi2,ψ

j
1

)]
= −

ℓ∑
k=0

c2ℓ+1
2k ∂2ℓ−2k+1

x

{[
δi ∧ ∂2kδj − δj ∧ ∂2kδi

]
(ψ1,ψ2)

}
,

i.e.

δi ∧ ∂2ℓ+1δj − δj ∧ ∂2ℓ+1δi =−
ℓ∑

k=0

c2ℓ+1
2k ∂2ℓ−2k+1

x

[
δi ∧ ∂2kδj − δj ∧ ∂2kδi

]
. (249)

Equations (248) and (249) are the generalization of the (d1=1 dimensional version of)
equation (68) to higher dimensions d2 and orders in derivation.

We can now decompose on the basis (78) the sum over the Sγ
(2ℓ)
ijx in equation (246)

and rearrange the terms as follows:

bq/2c∑
ℓ=0

Sγ
(2ℓ)
ijx

[
δix ∧ ∂2ℓδjx+ δjx ∧ ∂2ℓδix

]
=

bq/2c∑
ℓ=0

ℓ−1∑
k=0

b2ℓ2k+1

[
∂2ℓ−2k−1
x

(
Sγ

(2ℓ)
ijx

)][
δi ∧ ∂2k+1δj + δj ∧ ∂2k+1δi

]
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=

bq/2c−1∑
k=0

bq/2c∑
ℓ=k+1

b2ℓ2k+1

[
∂2ℓ−2k−1
x

(
Sγ

(2ℓ)
ijx

)][
δi ∧ ∂2k+1δj + δj ∧ ∂2k+1δi

]
=

b(q−1)/2c∑
ℓ=0

bq/2c∑
k=ℓ+1

b2k2ℓ+1

[
∂2k−2ℓ−1
x

(
Sγ

(2k)
ijx

)][
δi ∧ ∂2ℓ+1δj + δj ∧ ∂2ℓ+1δi

]
.

To get the first equality above, we used equation (248) and integrated by parts several
times. The second equality is then obtained by permuting the two sums, while the third
one comes from exchanging the dummy indices k↔ ℓ and replacing the upper bound of
the first sum by b(q− 1)/2c⩾ bq/2c− 1, which is harmless since, when this inequality
is strict, the second sum is empty. Using equation (249), we can perform the same

calculation with the sum over the Aγ
(2ℓ+1)
ijx in equation (246):

b(q−1)/2c∑
ℓ=0

Aγ
(2ℓ+1)
ijx

[
δix ∧ ∂2ℓ+1δjx− δjx ∧ ∂2ℓ+1δix

]
=

b(q−1)/2c∑
ℓ=0

ℓ∑
k=0

c2ℓ+1
2k

[
∂2ℓ−2k+1
x

(
Aγ

(2ℓ+1)
ijx

)][
δi ∧ ∂2kδj − δj ∧ ∂2kδi

]
=

b(q−1)/2c∑
k=0

b(q−1)/2c∑
k=ℓ

c2ℓ+1
2k

[
∂2ℓ−2k+1
x

(
Aγ

(2ℓ+1)
ijx

)][
δi ∧ ∂2kδj − δj ∧ ∂2kδi

]
=

bq/2c∑
ℓ=0

b(q−1)/2c∑
ℓ=k

c2k+1
2ℓ

[
∂2k−2ℓ+1
x

(
Aγ

(2k+1)
ijx

)][
δi ∧ ∂2ℓδj − δj ∧ ∂2ℓδi

]
.

Injecting these expressions back into equation (246) and rearranging the (implicit)
sums over i,j = 1, . . . ,d2 using the symmetry of the corresponding terms, we get formu-
las (75)–(77), from which we deduce that the family (78) indeed generates the space
Ω2

loc(F).

E.2. A free family of local 2-forms

The objective of this subsection is to show that the family (78) of functional 2–forms

is free in the following sense: if there exist smooth functions α
(k)
ij (x) and β

(k)
ij (x) on R

such that ∑
1⩽i<j⩽d2

∑
k

ˆ
dx α

(k)
ij (x)

[
δix ∧ ∂2kδjx− δjx ∧ ∂2kδix

]
+

∑
1⩽i⩽j⩽d2

∑
k

ˆ
dx β

(k)
ij (x)

[
δix ∧ ∂2k+1δjx+ δjx ∧ ∂2k+1δix

]
= 0 , (250)

where the sums over k are finite, then the functions α
(k)
ij and β

(k)
ij are all identically zero.

Note that our notions of ‘generative’ and ‘free’ for a family of vectors (here elements of
Ω2(F)) slightly vary from the usual ones in which linear combinations are always finite,
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whereas here the sums over discrete indices are finite, but we also integrate (i.e. ‘sum
over infinitely many terms’) over the continuous variable x.

Let us start by denoting by ω the 2–form on the left–hand side of equation (250). The

functions α
(k)
ij (respectively βij(k)) are only defined for 1⩽ i < j ⩽ d2 ( 1⩽ i ⩽ j ⩽ d2

respectively). For 1⩽ j ⩽ i ⩽ d2, we define α
(k)
ij ≡−α(k)

ji and β
(k)
ij ≡ β

(k)
ji . Equation (250)

then means that for any pair of functions (ψ1,ψ2) from R to Rd2:

ω (ψ1,ψ2) = 0 , (251)

with

ω (ψ1,ψ2) =

d2∑
i,j=1

∑
k

ˆ
dx α

(k)
ij (x)

[
ψix1 ∂

2kψjx2 −ψix2 ∂
2kψjx1

]

−
d2∑

i,j=1

∑
k

ˆ
dx β

(k)
ij (x)

[
ψix1 ∂

2k+1ψjx2 −ψix2 ∂
2k+1ψjx1

]
. (252)

Let us denote by ψ̂ℓ (respectively by α̂
(k)
ij and β̂

(k)
ij ) the Fourier transform of ψℓ (respect-

ively of α
(k)
ij and β

(k)
ij ) with the following convention:

ψiℓ (x) =

ˆ
ψ̂iℓ (p)e

2iπ pxdp , (253)

and similarly for the α
(k)
ij and β

(k)
ij . We can then rewrite ω(ψ1,ψ2) as follows

ω (ψ1,ψ2) =

d2∑
i,j=1

∑
k

ˆ
dxdpdq α

(k)
ij (x)e2iπ(p+q)x

[
ψ̂ip1 ψ̂

jq
2 (2iπ q)2k− ψ̂iq2 ψ̂

jp
1 (2iπ p)2k

]

−
d2∑

i,j=1

∑
k

ˆ
dxdpdq β

(k)
ij (x)e2iπ(p+q)x

[
ψ̂ip1 ψ̂

jq
2 (2iπ q)2k+1− ψ̂iq2 ψ̂

jp
1 (2iπ p)2k+1

]
.

(254)

We now choose ψ1,ψ2 such that ψ̂i1(p) = δi,mδ(p− p0) and ψ̂
i
2(q) = δi,nδ(q− q0). We thus

have

ω (ψ1,ψ2) =
∑
k

(2iπ)2k
[
p2k0 + q2k0

]
α̂
(k)
ij (−p0− q0)

+
∑
k

(2iπ)2k+1 [p2k+1
0 − q2k+1

0

]
β̂
(k)
ij (−p0− q0) . (255)

Upon defining

r ≡ p0+ q0 , s≡ p0− q0 , (256)
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together with the polynomials

Pk,r (s)≡ (r+ s)2k+(r− s)2k and Qk,r (s)≡ (r+ s)2k+1− (r− s)2k+1 . (257)

Equation (255) reads

ω (ψ1,ψ2) =
∑
k

(iπ)2k α̂
(k)
ij (−r)Pk,r (s)+

∑
k

(iπ)2k+1 β̂
(k)
ij (−r)Qk,r (s) . (258)

The assumption (251) implies that the right–hand side of equation (258) vanishes for all
r,s ∈ R. But the family of polynomials (in the s variable) (Pk,r(s),Qk,r(s))k∈N is clearly
free (since it is staggered in degree). Thus, we have

∀r ∈ R , α̂
(k)
ij (−r) = β̂ij(k) (−r) = 0 , (259)

i.e. the Fourier transforms of the α
(k)
ij ’s and βij(k)’s are identically zero, hence these

functions are themselves identically vanishing.
Note that this result can be straightforwardly generalized to the family (88) in

dimension d1 > 1. Indeed, repeating the same steps as above, we get to an equation
similar to (258) where the polynomials Pk,r(s) and Qk,r(s) are respectively replaced by
polynomials Pk,rn(sn) and Qk,rn(sn), with a sum over n= 1, . . . ,d1. We can eventually
conclude by the same argument since the variables sn, n= 1, . . . ,d1 are independent.

Appendix F. Decomposition of antisymmetric operators

In this appendix we prove formulas (100) and (101) of section 4.3 in the main text. To
this end, let us associate to any x -dependent square matrix M(x) = (Mij)i,j=1,...,d2 the
differential operators PA

k [M] and PS
k [M], for any k ∈ N, that each map an Rd2-valued

function ϕ(x) over R to another one, respectively given by

[
PA
k [M]ϕ

]
i
≡

d2∑
j=1

(
Mij∂

k
xϕj − (−1)k ∂kxMijϕj

)
, (260)

and

[
PS
k [M]ϕ

]
i
≡

d2∑
j=1

(
Mij∂

k
xϕj +(−1)k ∂kxMijϕj

)
. (261)

Taking the L2-scalar product of PS/A
k [M]ϕ with another Rd2-valued function ψ(x) and

performing k integrations by parts gives the relationsˆ
ψ · PS/A

k [M]ϕ≡
∑
i

ˆ
ψi (x)

[
PS/A
k [M]ϕ

]
i
(x)dx

=
∑
i,j

ˆ
Mij (x)DS/A

k (ϕj,ψi)(x)dx , (262)
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where DS
k is defined in appendix D. Hence, using relation (262) together with decom-

positions (242) and (243) and performing integrations by parts, we get on the one hand

ˆ
ψ · PA

2k [M]ϕ=
∑
i,j

ˆ
Mij

k−1∑
ℓ=0

b2k2ℓ+1∂
2k−2ℓ−1
x DA

2ℓ+1 (ϕj,ψi)

=
∑
i,j

k−1∑
ℓ=0

b2k2ℓ+1 (−1)2k−2ℓ−1
ˆ (

∂2k−2ℓ−1
x Mij

)
DA

2ℓ+1 (ϕj,ψi)

= −
ˆ
ψ ·

{
k−1∑
ℓ=0

b2k2ℓ+1PA
2ℓ+1

[
∂2k−2ℓ−1
x M

]}
ϕ

and on the other hand

ˆ
ψ · PS

2k+1 [M]ϕ=
∑
i,j

ˆ
Mij

k∑
ℓ=0

c2k+1
2ℓ ∂2k+1−2ℓ

x DS
2ℓ (ϕj,ψi)

=
∑
i,j

k∑
ℓ=0

c2k+1
2ℓ (−1)2k+1−2ℓ

ˆ (
∂2k+1−2ℓ
x Mij

)
DS

2ℓ (ϕj,ψi)

= −
ˆ
ψ ·

{
k∑
ℓ=0

c2k+1
2ℓ PS

2ℓ

[
∂2k+1−2ℓ
x M

]}
ϕ .

Since these relations are valid for all functions ϕ,ψ, we conclude that

PA
2k [M] =−

k−1∑
ℓ=0

b2k2ℓ+1PA
2ℓ+1

[
∂2k−2ℓ−1
x M

]
(263)

and

PS
2k+1 [M] =−

k∑
ℓ=0

c2k+1
2ℓ PS

2ℓ

[
∂2k+1−2ℓ
x M

]
, (264)

from which we deduce, in turn, formulas (100) and (101) that we wanted to prove.

Appendix G. Phenomenology of the basis of vorticities for d 1 = 1

In this appendix we successively study the phenomenology associated with elements
of the antisymmetric and symmetric subfamilies by using the vorticity dynamics (47),
restricting to the case where the diffusion operator D is the identity.
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G.1. The antisymmetric family

We first define

U ≡
[
ρ1 cos(θ1)
ρ2 cos(θ2)

]
and V ≡

[
−ρ2 sin(θ2)
ρ1 sin(θ1)

]
. (265)

In what follows, for any vector Z = (Z1,Z2)
> ∈ R2, we denote by Z⊥ the vector Z rotated

by π/2 clockwise, i.e. Z⊥ = (−Z2,Z1)
>. Then, using trigonometric identities, we decom-

pose δϕk(t= 0) as a superposition of circularly polarized harmonics:

δϕk (0)≡
[
ρ1 cos(kx+ θ1)
ρ2 cos(kx+ θ2)

]
(266)

=

[
ρ1 (coskxcosθ1− sinkxsinθ1)
ρ2 (coskxcosθ2− sinkxsinθ2)

]
(267)

= U coskx+V ⊥ sinkx (268)

=
U +V

2
coskx+

(
U +V

2

)⊥

sinkx (269)

+
U −V

2
coskx−

(
U −V

2

)⊥

sinkx . (270)

But for Wk given by equation (110), for any vector Z ∈ R2, we have:

etWk
(
Z coskx±Z⊥ sinkx

)
= (cosWktcoskx∓ sinWktsinkx)Z (271)

+ (sinWktcoskx± cosWktsinkx)Z
⊥ (272)

= cos(kx±Wkt)W ± sin(kx±Wkt)Z
⊥ , (273)

i.e. the operator t→ etWk translates in opposite directions circular waves that are polar-
ized in opposite senses.

Hence

δϕk (t) = etWkδϕk (0) (274)

=
U +V

2
cos(kx+Wkt)+

(
U +V

2

)⊥

sin(kx+Wkt) (275)

+
U −V

2
cos(kx−Wkt)−

(
U −V

2

)⊥

sin(kx−Wkt) . (276)
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Finally, upon defining ρ± and θ± the norm and angle (with respect to e1 = (1,0)>) of
(U ±V )/2 respectively, the solution finally reads in the canonical basis:

δϕk (t) = ρ+

[
cos(kx+Wkt+ θ+)
sin(kx+Wkt+ θ+)

]
+ ρ−

[
cos(kx−Wkt− θ−)
−sin(kx−Wkt− θ−)

]
, (277)

where, in particular, ρ± are given by

ρ± =
1

2

[
ρ21+ ρ22± 2ρ1ρ2 sin(θ1− θ2)

]1/2
. (278)

G.2. The symmetric family

We first set

δϕ̃k (t)≡ c(t)eikx , (279)

where c(t) = (c1(t),c2(t))
> and (e1,e2) denotes the canonical basis of R2. Upon denoting

by (λ1,λ2) the eigenvalues of β(ℓ) and (b1,b2) the associated orthonormal eigenvectors,

the solution of dynamics ∂tδϕ̃k =Wδϕ̃k, with W= β(ℓ)∂2ℓ+1, reads

δϕ̃k (x, t) = ei(kx+W
j
k t) (c(0) ·bj)bj , with W j

k ≡ (−1)ℓk2ℓ+1λj . (280)

Now if we denote by R the transition matrix between basis b and e, i.e. bi =Rjiej,
and assume that cj(0) = ρje

iθj , then

δϕ̃k (x, t) = ρme
i(kx+W j

k t+θm)Rmjbj . (281)

Taking the real part finally leads to the solution

δϕk (x, t) = ρm cos
(
kx+W j

k t+ θm

)
Rmjbj , (282)

with initial condition δϕk(x,0) = [ρ1 cos(kx+ θ1),ρ2 cos(kx+ θ2)]
>.

We now assume that β(ℓ) reads

β(ℓ) = β
(ℓ)
12

[
0 1
1 0

]
. (283)

Its eigenvalues are λ1 = β
(ℓ)
12 ,λ2 =−β(ℓ)

12 and respective eigenvectors are b1 = (1,1)>/
√
2

and b2 = (1,−1)>/
√
2. In this case, solution (281) is thus

δϕ̃k (x, t) =
1

2

{
ρ1e

i(kx+W 1
k t+θ1) + ρ2e

i(kx+W 1
k t+θ2)

}[
1
1

]
(284)

+
1

2

{
ρ1e

i(kx+W 2
k t+θ1)− ρ2e

i(kx+W 2
k t+θ2)

}[
1
−1

]
, (285)
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i.e.

δϕ̃k (x, t) = ρ+ei(kx+W
1
k t+θ

+)
[
1
1

]
+ ρ−ei(kx+W

2
k t+θ

−)
[
1
−1

]
, (286)

with moduli ρ± and phases θ± such that

ρ±eiθ
± ≡ ρ1e

iθ1 ± ρ2e
iθ2

2
. (287)

Noting that W 2
k =−W 1

k and taking the real part then gives the solution

δϕk (x, t) = ρ+ cos
(
kx+W 1

k t+ θ+
)[1

1

]
+ ρ− cos

(
kx−W 1

k t+ θ−
)[ 1

−1

]
, (288)

with initial condition δϕk(x,0) = [ρ1 cos(kx+ θ1),ρ2 cos(kx+ θ2)]
>, and where, in par-

ticular, ρ± are given by

ρ± =
1

2

[
ρ21+ ρ22± 2ρ1ρ2 cos(θ1− θ2)

]1/2
. (289)

Appendix H. Non-reciprocal flocking

H.1. Active polar mixture

In [38], the authors study a mixture of two species (A,B) of active Brownian particles
undergoing (anti-)aligning interactions in two dimensions. Starting from a microscopic
dynamics, they then perform an explicit coarse-graining to obtain a hydrodynamic
description for the density and polarization fields of each species ρA,B,PA,B. They show
that the system can be in several phases: disordered, aligned, antialigned, chiral, swap,
or a mix between the latter two that they call the chiral+swap phase. In order to
analyze the transitions between these phases, they focus on the case where all the
order-parameter fields are homogeneous in space. Their hydrodynamics then reduces to
two equations over the polarity fields:

∂tPA =

[
jAAρA− η− 1

2η
‖jAAPA+ jABPB‖2

]
PA+ jABρAPB (290)

∂tPB =

[
jBBρB − η− 1

2η
‖jBBPB + jBAPA‖2

]
PB + jBAρBPA , (291)

where ρA and ρB are the respective homogeneous densities of each species, η the squared
amplitude of the microscopic angular noise, and (jαβ) the matrix of the (renormalized)
alignment constants. Still neglecting the gradient terms in the hydrodynamics originally
derived in [38], we add random fields to the above equations to account for fluctuations
in a simple way:
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∂tPA =

[
jAAρA− η− 1

2η
‖jAAPA+ jABPB‖2

]
PA+ jABρAPB +ΛA (292)

∂tPB =

[
jBBρB − η− 1

2η
‖jBBPB + jBAPA‖2

]
PB + jBAρBPA+ΛB , (293)

where ΛA(r, t) and ΛB(r, t) are independent Gaussian fields, each having the same
statistics as η in equation (8). Note that another possibility to implement fluctuations,
(which is perhaps a little more coherent with the fact that we neglected the gradient
terms of the original hydrodynamics) would have been to consider uniform noise fields,
in which case the problem would have been reduced to a finite-dimensional one (see our
paper I [15] for the corresponding tools). Interestingly, the resulting finite-dimensional
vorticity ω̄ is related to the one studied below for non-uniform random field, ω, as
follows:

ω (δPA,δPB) =

ˆ
ω̄ (δPA (r) ,δPB (r))dr . (294)

Since we here aim at illustrating the use of our field-theoretic methods, below we stick
to the case of the non-uniform random fields of equations (292)–(293).

As shown in [38], when jAB 6= jBA and η is sufficiently small, the polarizations of the
two species undergo an ‘angular run and chase’ dynamics, that can either take the form
of a chiral phase, a swap phase, or a chiral+swap phase. Here we want to show that
these phenomenologies can be heuristically inferred from the vorticity dynamics (47)
associated to equations (292)–(293).

As the operator that is denoted by b in the generic dynamics (8) is here the identity,
the diffusion operator D= bb† is also the identity operator. Let us now compute the
vorticity two-form ω ≡ dD−1a of the dynamics, where a(r, [PA,PB]) is a R4-valued field
over R2 obtained by stacking together the deterministic parts on the right-hand side of
equations (292) and (293).

ω =
∑

α,γ=A,B

2∑
i,k=1

ˆ
drdr ′


jααρα− η− 1

2η

∣∣∣ ∑
β=A,B

jαβP
r
β

∣∣∣2
 δP ir

α

δP kr ′
γ

δγkr
′ ∧ δαir

−1

η

2∑
l=1

 ∑
β=A,B

jαβP
lr
β

 ∑
µ=A,B

jαµ
δP lr

µ

δP kr ′
γ

P ir
α δ

γkr ′ ∧ δαir


+
∑
γ=A,B

2∑
i,k=1

ˆ
drdr ′

[
jABρA

δP ir
B

δP kr ′
γ

δγkr
′ ∧ δAir+ jBAρB

δP ir
A

δP kr ′
γ

δγkr
′ ∧ δBir

]

= − 1

η

∑
α,γ

∑
i,l

ˆ
dr

∑
β

jαβP
lr
β

jαγP ir
α δ

γlr ∧ δαir

+
∑
i

ˆ
dr
[
jABρAδ

Bir ∧ δAir+ jBAρBδ
Air ∧ δBir

]
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where we used δP ir
α

δP kr ′
γ

= δα,γδ
i,kδ(r− r ′) together with δαir ∧ δαir = 0, the latter stemming

from the antisymmetry of the wedge product. As we now have integrals over r only,
we can safely drop the variable r everywhere to lighten notations. Using again the
antisymmetry of the wedge product, we get∑

α,γ

∑
i,l

jαβjαγP
l
βP

i
α δ

γl ∧ δαi = 1

2

∑
α,γ

∑
i,l

[
jαβjαγP

l
βP

i
α− jγβjγαP

i
βP

l
γ

]
δγl ∧ δαi ,

so that the vorticity two-form reads

ω = − 1

2η

∑
α,γ,β

∑
i,l

ˆ [
jαβjαγP

l
βP

i
α− jγβjγαP

i
βP

l
γ

]
δγl ∧ δαi

+
∑
i

ˆ [
jABρAδ

Bir ∧ δAir+ jBAρBδ
Ai ∧ δBi

]
.

Expanding the sums over α and γ, grouping the terms where α= γ and those where α 6=
γ, and using the antisymmetry of the wedge product, we get, after some rearrangement:

ω =
1

η

ˆ
det(PA,PB)

[
jABjAAδ

A1 ∧ δA2− jBAjBBδ
B1 ∧ δB2

]
+

1

η

∑
i,l

ˆ [
jAAjABP

i
AP

l
A+

(
j2AB − j2BA

)
P i
AP

l
B − jBBjBAP

i
BP

l
B

]
δAi ∧ δBl

−
∑
i

ˆ
[jABρA− jBAρB]δ

Ai ∧ δBi.

We first note that the vorticity two-form of dynamics (292)–(293) is entirely generated
by the antisymmetric subfamily of (78) of order ℓ= 0. To simplify the analysis of the phe-
nomenology associated with each component, we now assume that both self-interaction
terms are equal, jAA = jBB = j0, that the cross interaction is purely antisymmetric,
jAB =−jBA = j−, and that the species densities are equal, ρA = ρB = ρ0. The vorticity
then reduces to :

ω =
1

η

ˆ
det(PA,PB)j0j−

[
δA1 ∧ δA2+ δB1 ∧ δB2

]
+

1

η

∑
i,l

ˆ
j0j−

[
P i
AP

l
A+P i

BP
l
B

]
δAi ∧ δBl

−
∑
i

ˆ
2ρ0j−δ

Ai ∧ δBi . (295)

Let us decompose the vorticity two-form as ω = ω1+ω2+ω3, where ωi stands
for the ith line on the right-hand side of equation (295). Using the defini-
tion (39) of ω̂ together with relation (46), W=−Dω̂/2, the vorticity operator,
which acts on δϕ≡ (δP 1

A,δP
2
A,δP

1
B,δP

2
B)

> by multiplication, is readily shown to read
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W=W1+W2+W3, with:

W1 =
j0j−
2η

det(PA,PB)


0 −1 0 0
1 0 0 0
0 0 0 −1
0 0 1 0

 , (296)

W2 =
j0j−
2η

[
0 −

(
PAP

>
A+PBP

>
B

)
PAP

>
A+PBP

>
B 0

]
, (297)

W3 = ρ0j−


0 0 1 0
0 0 0 1
−1 0 0 0
0 −1 0 0

 , (298)

the operator W2 being defined by two-by-two blocks.
The contribution of W1 in the vortex dynamics (47) is clearly responsible for the

chiral phase reported in [38]: for instance if j− > 0 then the polarization of species
A ‘runs’ after that of species B which itself flees away, hence spontaneously breaking
spatial parity in R2 with an orientation that depends on the initial angle between the
two polarities. This collective rotation of PA and PB would occur at the angular speed
j0j−det(PA,PB)/2η, if W3 was the only term in the vorticity.

To interpret W1 and W2, let us consider a vector u in R2, and build from it the
two orthogonal vectors of R4 defined as U≡ (u,u)> and V≡ (−u,u)>. The operator
that generates rotations in the plane (U,V), at angular speed |U||V|= 2|u|2, and in
the direction U→V, reads

R≡VU>−UV> = 2

[
0 −uu>

uu> 0

]
. (299)

The dynamics ∂tδϕ=Rδϕ, where ϕ= (δP>
A,δP

>
B), follows a circular orbit in R4 which

start at δϕ(0) and passes, at a time equal to a quarter of its period, by the point
δϕ(T/4). In the latter, the projections of δPA(T/4) and δPB(T/4) along u⊥ are the
same as initially (they are invariant under the dynamics) while the their projections on u
are given by −δPB(0) and δPA(0), respectively. This phenomenology closely resembles
that of the swap phase reported in [38], and the operator W2 (respectively W3) is
a superposition of two such rotation generators respectively along PA and PB (along
(1,0)> and (0,1)>, respectively).

Appendix I. Active Ising model

In this appendix, we compute the vorticity two-form and operator of the AIM.
We introduce slightly different notation here: the functional one-forms ∂kδmx are

now denoted by (−1)k∂kδmx, and similarly for the field ρ. This allows getting rid of the
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powers of −1 that appear when using derivatives of Dirac deltas. Indeed, if δϕ≡ (δρ,δm)
is a perturbation, we simply have

∂kδmx (δϕ) = ∂kδmx , (300)

rather than

∂kδmx (δϕ) = (−1)k ∂kδmx . (301)

The main risk is now to make the confusion between functional forms and perturbations.
For instance δρx ∧ δmx is not some sort of cross product between the two components of
a perturbation δϕ= (δρ,δm), but a bilinear map that associates to a pair of fluctuations
δϕ1 = (δρ1,δm1), δϕ2 = (δρ2,δm2) the number δρx1δm

x
2 − δρx2δm

x
1 . Finally, we adopt the

generalized Einstein convention that consist in integrating over repeated continuous
indices, with any subscript of a partial symbol ∂ being excluded from this convention, as
we only keep them in the calculation to remember with respect to which variable we
take derivatives.

Let us now turn to the AIM (131) and (132). The noise being additive, the spurious
drift vanishes, so that the drift a of the generic dynamics (8) reads in this case

a=

[
D∂2xρ− v∂xm

D∂2xm− v∂xρ+ γ1m+ γ2m
3

]
, (302)

while the diffusion operator is

D=

[
−D∂2x 0

0 D

]
. (303)

Denoting by Gxy ≡G(x− y) the Green function of the 1d Laplacian, i.e. ∂2xG(x− y) =
δ(x− y), the one form D−1a reads

D−1a=
(
−ρx+

v

D
Gxz∂zmz

)
δρx+

(
∂2xmx−

v

D
∂xρx+

γ1
D
mx+

γ2
D
m3
x

)
δmx . (304)

We now apply formula (32) to compute the vorticity two-form ω ≡D−1a of the AIM:

ω = d
(
−ρx+

v

D
Gxz∂zmz

)
∧ δρx+ d

(
∂2xmx−

v

D
∂xρx+

γ1
D
mx+

γ2
D
m3
x

)
∧ δmx

=
δ

δρy

(
−ρx+

v

D
Gxz∂zmz

)
δρy ∧ δρx+ δ

δmy

(
−ρx+

v

D
Gxz∂zmz

)
δmy ∧ δρx

+
δ

δρy

(
∂2xmx−

v

D
∂xρx+

γ1
D
mx+

γ2
D
m3
x

)
δρy ∧ δmx

+
δ

δmy

(
∂2xmx−

v

D
∂xρx+

γ1
D
mx+

γ2
D
m3
x

)
δmy ∧ δmx .
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Computing the functional derivatives and using the fact that δρx ∧ δρx = δmx ∧ δmx = 0
because the wedge product is antisymmetric, we get

ω =
v

D
Gxz∂zδ (y− z)δmy ∧ δρx+

[
∂2xδ (x− y)

]
δmy ∧ δmx (305)

− v

D
[∂xδ (x− y)]δρy ∧ δmx+

γ ′
2

D
m3
xδ (x− y)δρy ∧ δmx , (306)

where γ ′
2 ≡ d

dργ2. Proceeding to several integrations by parts and integrating out the

Dirac deltas, we finally get:

ω =
v

D
δρx ∧ ∂δmx− v

D
Gxyδρ

x ∧ ∂δmy +
γ ′
2

D
m3
xδρ

x ∧ δmx . (307)

In order to get the associated vorticity operator W, we first determine the cycle affinity
operator ω̂, defined as (39). To this purpose, we apply ω to a pair δϕ1,δϕ2 of perturb-
ations, integrate by parts every derivative that applies to δϕ1, and change integration
variables. We can then factorize δϕ1 and identify ω̂ as the resulting operator that acts
on δϕ2 only:

ω (δϕ1,δϕ2) =
v

D
(δρx1∂δm

x
2 − δρx2∂δm

x
1)−

v

D
Gxy (δρ

x
1∂δm

y
2 − δρx2∂δm

y
1)

+
γ ′
2

D
m3
x [δρ

x
1δm

x
2 − δρx2δm

x
1 ]

= δρx1

[
v

D
(∂δmx

2 −Gxy∂m
y
2)+

γ ′
2

D
m3
xδm

x
2

]
+ δmx

1

[
v

D
∂δρx2 −

v

D
∂xGyxδρ

y
2 −

γ ′
2

D
m3
xδρ

x
2

]
.

Hence, the cycle-affinity operator, that applies to a perturbation δϕ(y), reads

ω̂ =

[
0 v

D (δ (x− y)−Gxy)∂y +
γ ′
2

Dm
3
xδ (x− y)

v
D∂xδ (x− y)− v

D∂xGyx− γ ′
2

Dm
3
xδ (x− y) 0

]
(308)

and is antisymmetric as expected. Consequently, the vorticity operator, which satisfies
W=−Dω̂/2, is given by

W=
1

2

[
0 vδ (x− y)

(
∂3y − ∂y

)
+ ∂2xγ

′
2m

3
xδ (x− y)

−v∂xδ (x− y)+ v∂xGyx+ γ ′
2m

3
xδ (x− y) 0

]
,

(309)

where we used the fact that ∂2xGxy = δ(x− y).
In the original coarse-grained ATM, γ2 depends on ρ(x) [49]. We see that this depend-

ence generates a term in ω along the antisymmetric family (the last one on the right-
hand side of (307)), which does not come from the self-propulsion but from the aligning
mechanism. As we are currently focusing on the symmetric family and self-propulsion
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effects, we assume from now on that γ2 is instead a constant. The vorticity operator
thus reduces to

W=
1

2

[
0 vδ (x− y)

(
∂3y − ∂y

)
−v∂xδ (x− y)+ v∂xGyx 0

]
. (310)

In Fourier space, W acts by multiplication by the matrix Wk given by:

Wk =
iv

2

[
0 k3+ k

k+1/k 0

]
(311)

where we used the facts that the Fourier transform39 turns G(x ) into Gk =−1/k2 and
a convolution into an usual product. The vectors v± ≡ (±k/

√
1+ k2,1

√
1+ k2)> are

eigenvectors of Wk for the eigenvalues λ± =±iv(1+ k2)/2. It follows that the solution
of the vorticity dynamics (47) in Fourier space is given by

δϕk (t) = 〈δϕk (0) |v+〉eλ+tv++ 〈δϕk (0) |v−〉eλ−tv− , (312)

where 〈·|·〉 denotes the canonical scalar product of C2. Injecting the expressions of v±
and λ± and rearranging the terms, we get

δϕk (t) =


2k2

1+k2 cos

(
vt(1+k2)

2

)
δρk (0)+

2ik
1+k2 sin

(
vt(1+k2)

2

)
δmk (0)

2ik
1+k2 sin

(
vt(1+k2)

2

)
δρk (0)+

2
1+k2 cos

(
vt(1+k2)

2

)
δmk (0)

 . (313)

We now take the inverse Fourier transform to get the real space solution of dynam-
ics (47):

δϕ(t) =

[
−K ′ ′ * fCF * δρ(0)−K ′ * fSF (t) * δm(0)
−K ′ * fSF * δρ(0)+K * fCF (t) * δm(0)

]
, (314)

where * stands for the convolution and the functions fCF(x, t) and fSF(x, t), which are
defined as

fCF (x, t)≡
1√
2πvt

sin

(
x2

2vt
− vt

2
+
π

4

)
(315)

and

fSF (x, t)≡
1√
2πvt

cos

(
x2

2vt
− vt

2
+
π

4

)
, (316)

are the inverse Fourier transform of cos(vt[1+ k2]/2) and sin(vt[1+ k2]/2), respectively.
In equation (314), K(x)≡ e−|x| is the inverse Fourier transform of 2

1+k2 (i.e. twice the

39 We choose the convention FT[f ](k) = f̂(k) =
´∞
−∞ f(x)eikxdx and FT−1[f̂ ](x) = 1

2π

´∞
−∞ f̂(k)e−ikxdk, where FT and FT−1

respectively stand for the Fourier transform and its inverse.
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Green function of the Screened Poisson equation, with unit screening constant), and K ′

and K ′′ are its derivatives.
As our main concern is whether the phenomenology of this dynamics, despite having

a non-local vorticity operator, is akin to that of the symmetric family for the local case
as defined in section 4.4.2, we consider an initial perturbation whose components are
harmonic waves of the same spatial frequency k which are either in phase or in phase
opposition :

δϕ(t= 0) =

[
δρ(0)
δm(0)

]
=Acos(kx+ θ)

[
1
ε

]
, (317)

where ε=1 (ε=−1) when the components are in phase (in phase opposition). In this
case, the solution (314) of the vorticity dynamics can be shown to read

δϕ(x, t) = δϕprop (x, t)+ δϕstat (x, t) , (318)

with

δϕprop (x, t) =
2

1+ k2
cos

(
kx+ ε

v
[
1+ k2

]
2

t+ θ

)[
εk
1

]
, (319)

and

δϕstat (x, t) =
2(k− 1)ε

1+ k2

k cos
(
v[1+k2]

2 t

)
cos(kx+ θ)

sin

(
v[1+k2]

2 t

)
sin(kx+ θ)

 . (320)

The component δϕstat of δϕ(x, t) is always a standing wave, while δϕprop propagates
either leftward or rightward depending on ε=±1, i.e. on whether the initial density
and polarity perturbations are in phase or in antiphase. If we were to play a video
of the time evolution of the graph of δϕ(x, t), we would see a traveling wave, whose
direction of propagation is the same as that of δϕprop, and whose amplitude and speed
seems to be modulated by its stationary component δϕstat. Thus, although non-local,
the vorticity operator generates a flow which is phenomenologically very close to that
of the symmetric family.

Appendix J. Loop–wise entropy production in the phase–separated AMB

In this appendix, we show that the entropy produced along the oriented loop C = ∂S ⊂
F, where S is parametrized by R : [0,1]× [0,2π/|w|]→ F whose expression is given in
equation (144), takes the form (145). Let us denote s= [0,1]× [0,2π/|w|]. We then use
equation (139) to compute the entropy production of dynamics (19) along ∂S via the
integral of ω over S =R(s):

Σ̂ [∂S] =
ˆ
S
ω =

ˆ
s

R*ω =

ˆ
s

ωR(τ ,t) (∂τR,∂tR)dτdt (321)
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where R* stands for the pullback by R (i.e. change of variables) and the last integral is
a usual two-dimensional integral on s. Using the expression (37) of the cycle affinity of
AMB, we get

Σ̂ [∂S] =
ˆ
s×R<0

dxdτdt [(2λ+κ ′)∂xρ] ∂xδ
x ∧ δx (∂τρ,∂tρ)

=

ˆ
s×R<0

dxdτdt (2λ+κ ′)∂xρ [−(∂x∂τρ)(∂tρ)+ (∂τρ)(∂x∂tρ)] .

But the derivatives of ρ(τ , t,x) with respect to τ and t respectively read

∂τρ(τ , t,x) =A(x)cos(kx−wt) , (322)

and

∂tρ(τ , t,x) =A(x)τw sin(kx−wt) . (323)

In turn, the entropy production along ∂S is

Σ̂ [∂S] =
ˆ
s×R<0

dxdτdt (2λ+κ ′) [∂xρss−Aτk sin(kx−wt)+A ′τ cos(kx−wt)]

×
[
−A ′Aτw cos(kx−wt)sin(kx−wt)+A2τwk sin2 (kx−wt)

+A ′Aτw cos(kx−wt)sin(kx−wt)+A2τwk cos2 (kx−wt)
]

=

ˆ
s×R<0

dxdτdt (2λ+κ ′) [∂xρss−Aτk sin(kx−wt)+A ′τ cos(kx−wt)]A2τwk

= wk
2π

|w|
1

2

ˆ
R<0

dx(2λ+κ ′)A2∂xρss

−
ˆ
[0,1]×R<0

A3τ 2wk2 (2λ+κ ′)∂xρss

ˆ 2π/|w|

0

dtsin(kx−wt)

+

ˆ
[0,1]×R<0

A ′A2τ 2wk

ˆ 2π/|w|

0

dtcos(kx−wt)

= sgn(w)kπ

ˆ
R<0

dx(2λ+κ ′)A2∂xρss ,

where we have just expanded the various products and integrated the sinusoidal func-
tions over one period 2π/|w| of the variable t. If we now assume that (2λ+κ ′) is
constant, we finally get

Σ̂ [∂S] = (2λ+κ ′)sgn(w)kπ

ˆ
R<0

dxA2∂xρss . (324)

This is the result used in section (5.1.3).
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Appendix K. Decomposition of the current, hidden current, and hidden IEPR

K.1. Joint IEPR of the field and its current

For a given solution (ϕt, jt)t of dynamics (150) and (151), we introduce the Rd4-valued
field:

qt ≡ q0+

ˆ t

0

jsds , (325)

with q0 such that Bq0 = ϕ0. Time integrating equation (150) gives

ϕt =Bqt , (326)

which allows to see j,J,s, and h directly as functionals of q. In turn, this allows the
rewriting of equation (150) and (151) as a closed random dynamics over the field q:

∂tq= J+ s+ h+ bη . (327)

The crucial point is now that s and hλ respectively coincide with the Stratonovitch-
spurious drift and the λ-gauge associated with the dynamics of (327). Indeed, adapting
the general formula (10) to dynamics (327) gives the Stratonovitch spurious drift:

bi1r1i3r3

δ

δqi2r2
bi2r2i3r3

= bi1r1i3r3

δϕi4r4

δqi2r2
δ

δϕi4r4
bi2r2i3r3

= bi1r1i3r3
Bi4r4
i2r2

δ

δϕi4r4
bi2r2i3r3

= bi1r1i3r3

δ

δϕi4r4
bi4r4i3r3

= si1r1 ,

where we used the chain rule to get the first equality, relation (326) to go from the first
to the second line, relation (147) together with the fact that B is independent of ϕ
to get to the third, and the definition of s to conclude. A very similar calculation also
shows the coincidence between hλ and the λ-gauge drift of dynamics (327).

We can now deduce that the joint (Stratonovitch) path-probability P[(ϕt,qt)t∈T]
reads

P [(ϕt,qt)t] = P [(ϕt)t |(qt)t]P [(qt)t]

∝ δ [(ϕt−Bqt)t] exp

{
−1

4

ˆ T

0

(∂tqt−Jt)
[
bb†
]−1

(∂tqt−Jt)dt

}
,

up to a multiplicative factor that will be irrelevant to compute the IEPR. Note that,
in the last equation, the dagger stands for the adjoint with respect to the canonical
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L2 scalar product. Making the change of variable (qt)t∈T → (jt = ∂tqt)t∈T in the path
integral gives the joint path-probability40

P
[
(ϕt, jt)t∈T

]
∝ δ [(∂tϕt−Bjt)t] exp

{
−1

4

ˆ T

0

(jt−Jt)
[
bb†
]−1

(jt−Jt)dt

}
. (328)

We can finally deduce the IEPR associated to the pair (ϕ, j) of variables:

σϕ,j ≡ lim
T →∞

1

T
ln

P
[
(ϕt, jt)t∈T

]
P
[(
ϕT −t,−jT −t

)
t∈T

] =〈ˆ j
[
bb†
]−1

Jdr

〉
. (329)

K.2. Hidden current

In this section we prove the decomposition (164) of the space of currents in the case of
section 5.2.2:

Jρ = Im(−M∇)⊕ ker(∇·) , (330)

before briefly discussing the general decomposition (155) of section 5.2.1.
Let us start by recalling that, according to Helmholtz-Hodge theory [55], if g ij is

a Riemannian metric on Rd1, then the space of (square-integrable) vector fields over
this space (that we here assimilate to Jρ, for a fixed ρ) can be decomposed as the
superposition of the image of the Riemannian gradient and the kernel of the corres-
ponding divergence. This means that, for a given vector field u(r) over Rd1, there exists
a scalar potential µ(r) and a vector field γ(r) whose Riemannian divergence vanishes,
i.e. ν−1∂i (νγ

i) = 0, with ν =
√

det(gij) the corresponding Riemannian volume element,
which are such that

ui =−gij∂jµ+ γi , (331)

where g ij is the dual metric, satisfying gijgjk = δik.
Let us now suppose that d1 6= 2 and define the metric tensor

gij = (detM)1/(d1−2) [M−1
]
ij

. (332)

Then, for a given current J(r) over Rd1, we set

u≡ J/ν , (333)

40 The rigorous calculation requires a temporal discretization, and the change of variables is then between the variables (jndt)n and
(q(n+1/2)dt)n, with jndt ≡ (q(n+1/2)dt− q(n−1/2)dt)/dt. This change of variables make a Jacobian (that is a power of dt) and boundary
terms appear, all of which vanish when considering the ratio with the time-reversed path and the long-time limit in the calculation
of σϕ,j.
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where ν is the Riemaniann volume element associated to the metric (332). Hence, there
exist a scalar potential µ and a divergence-free vector field γ such that decomposi-
tion (331) holds for u given by (333). Then, note that

ν ≡
√
detgij

=
{
det
[
(detM)1/(d1−2) [M−1

]
ij

]}1/2

=
{
(detM)d1/(d1−2) (detM)−1

}1/2

= (detM)1/(d1−2) ,

while the dual metric reads

gij = (detM)−1/(d1−2)M ij . (334)

Thus J= νu splits as

J i =−M ij∂jµ+ γ̃i , (335)

where γ̃ ≡ νγ satisfies ∂i γ̃
i = ∂i(νγ

i) = 0, which is what we aimed at proving.
Let us now briefly discuss the decomposition

Jϕ = Im
(
bϕb

†
ϕB

†
)
⊕ ker(B) , (336)

that we assumed to hold in the general setting of section 5.2.1. We first denote by (·|·)0TϕF
and (·|·)0Jϕ the canonical L2-scalar product on TϕF and Jϕ, respectively. Then we define

another scalar product on the latter space:

(j1|j2)
1
Jϕ ≡

(
j1

∣∣∣∣[bϕb†ϕ]−1

j2

)0

Jϕ
=

ˆ
j1

[
bϕb

†
ϕ

]−1

j2dr . (337)

Then, it turns out bϕb
†
ϕB

† coincides with the adjoint of B with respect to the scalar

products (·|·)0TϕF in TϕF and (·|·)1Jϕ in Jϕ, which we denote by B*. Indeed, for any j ∈ Jϕ
and δϕ ∈ TϕF, using the definition of an adjoint operator, we have(

j|B*δϕ
)1
Jϕ

= (Bj|δϕ)0TϕF =
(
j|B†δϕ

)0
Jϕ

=
(
j|bϕb†ϕB

†δϕ
)1
Jϕ

. (338)

Thus, the splitting (336) is simply a decomposition of a space into the superposition of
the kernel of an operator and the image of its adjoint, and can consequently be expected
to occur rather generically, although a formal exploration of the conditions for it lies
beyond our scope here.
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